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Abstract: One of the fundamental problems in quantum gravity is to describe the experience
of a gravitating observer in generic spacetimes. In this paper, we develop a framework for
describing non-perturbative physics relative to an observer using the gravitational path
integral. We apply our proposal to an observer that lives in a closed universe and one that
falls behind a black hole horizon. We find that the Hilbert space that describes the experience
of the observer is much larger than the Hilbert space in the absence of an observer. In the case
of closed universes, the Hilbert space is not one-dimensional, as calculations in the absence of
the observer suggest. Rather, its dimension scales exponentially with G−1

N . Similarly, from
an observer’s perspective, the dimension of the Hilbert space in a two-sided black hole is
increased. We compute various observables probing the experience of a gravitating observer
in this Hilbert space. We find that an observer experiences non-trivial physics in the closed
universe in contrast to what it would see in a one-dimensional Hilbert space. In the two-sided
black hole setting, our proposal implies that non-perturbative corrections to effective field
theory for an infalling observer are suppressed until times exponential in the black hole
entropy, resolving a recently-raised puzzle in black hole physics. While the framework that we
develop is exemplified in the toy-model of JT gravity, most of our analysis can be extended
to higher dimensions and, in particular, to generic spacetimes not admitting a conventional
holographic description, such as cosmological universes or black hole interiors.
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1 Introduction

The description of cosmology and black hole interiors remains one of the most important
open problems in quantum gravity. The last few decades have seen significant progress in our
understanding of gravitational holography [1–5] and the gravitational path integral [6–28].
These techniques are especially suited for answering global questions that can be clearly
formulated from a boundary perspective. Examples include correlation functions between
boundary points and entanglement entropies of subsystems in the dual theory [29–32]. On
the other hand, it is often unclear how to describe the local experience of an observer that,
like us, is part of the gravitational spacetime. This is particularly true for observers falling
into black holes [33–39] or observers in spacetimes that do not have asymptotic boundaries,
for example in cosmology [8, 11, 40–61]. This is an obstacle that we need to overcome if we
are to achieve a description of quantum gravity that explains our own experience.

In recent years, progress has been made towards understanding the experience of observers
in gravitating spacetimes [56, 62–73] but these approaches have not incorporated non-
perturbative quantum gravity effects into their descriptions of local physics experienced
by the observer. These effects, which are captured by the gravitational path integral and
holography, are critical to calculating various properties of the quantum gravity Hilbert
space and the observables defined on it [13, 16, 17, 26, 27, 37–39, 74, 75]. It is plausible
that they also play a role in describing physics experienced by an observer, but no concrete
proposal exists for a non-perturbative treatment of this issue. The goal of this paper is to
present such a proposal. We use the gravitational path integral to determine properties of
the non-perturbative quantum gravity Hilbert space needed to describe the experience of a
gravitating observer and to study the observables that such an observer could measure.

Our proposal is motivated by several shortcomings of the current approach to the
gravitational path integral when describing the experience of an observer. An important
example is the physics of closed universes. The inner products between different closed
universe states computed by the gravitational path integral have large fluctuations due to
non-perturbative effects [11, 54, 75–77], signaling a drastic breakdown of effective field theory.
Notably, even inner products between states in which an observer exists and states in which
it does not are O(1), a fact signaled by large statistical fluctuations in these inner-products.
Therefore, the observer itself is not well-defined at all times. This is troublesome because we
need a well-defined notion of an observer not subject to large fluctuations in order to describe
physics from its point of view. A further drastic consequence of these large fluctuations is
that the quantum gravity Hilbert space for a closed universe is one-dimensional [11, 76, 78].
This result is problematic if our goal is to describe the experience of an observer living in a
closed universe, because a local observer in a closed universe should experience non-trivial
physics. In fact, experimental data do not rule out the possibility that we are living in a
closed universe [79–81], and our local experience should be unaffected by the global properties
of the universe. Therefore, an observer should have access to a much larger Hilbert space than
the one-dimensional Hilbert space suggested by the gravitational path integral arguments.

A non-perturbative description of an observer’s experience is also necessary to address
the long-standing issue regarding the fate of an observer falling into a black hole [33–39].
This is particularly important for very old black holes, for which non-perturbative effects are
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Figure 1. Our proposal for the gravitational path integral in the presence of an observer. The
worldline of the observer (depicted in red) must connect a bra and the corresponding ket when
computing moments of an overlap ⟨ψi|ψj⟩n. This rule can be seen as an additional boundary condition
to impose when summing over geometries. (a) The overlap ⟨ψi|ψj⟩ between two closed universe states
in pure JT gravity is unaffected by our new rules. (b) The square of an overlap |⟨ψi|ψj⟩|2 between
closed universe states. The gravitational path integral sums over all possible geometries satisfying the
boundary conditions at the asymptotic boundaries and at the worldline of the observer. We depict here
the leading disconnected contribution and the first subleading term, a genus-zero connected geometry.

expected to give large corrections to effective field theory. Various proposals have attempted
to quantify how effective field theory fails [37–39], but none of them develop the framework
that understands the problem in the Hilbert space relevant for describing the experience
of the infalling observer.

We propose to compute inner-products and their moments using the gravitational path
integral while imposing that the observer of interest always exists between the bra and the
ket. Consider an initial and a final slice on which the boundary conditions associated with
the bra and the ket are defined. In our proposal, only geometries for which there is a foliation
continuously interpolating between these two slices in which the observer is present on every
slice contribute to the gravitational path integral. We shall motivate our proposal by showing
that, among other benefits, it excludes non-physical contributions to transition probabilities.
This prescription allows us to compute transition probabilities in the presence of the observer
as well as compute observables dressed to the observer’s worldline. In practice, our proposal
can be achieved by requiring that, when computing moments of a given overlap, the observer’s
worldline always connects a given bra to the corresponding ket, see e.g. figure 1, whereas
other matter worldlines are allowed to connect arbitrary bras and kets. This prescription
should be contrasted with the usual rules for the global gravitational path integral, in which
worldlines associated with all operator insertions, including those creating and annihilating
an observer, can connect between arbitrary bras and kets.1

We emphasize that our proposal is relevant when asking questions related to the experience
of a given gravitating observer. We are building Hilbert spaces that describe physics with
respect to some subsystem. This justifies a different prescription for the observer’s worldvolume
compared to other operator insertions. We decide which worldvolumes to treat in this way
based on the quantities we are interested in computing. For example, to capture the experience
of two bulk observers in 2D gravity, both of their worldlines would need to connect bras to their

1Notice that this prescription for the gravitational path integral, which we will review in section 2, is
precisely what causes large fluctuations in the inner product between closed universe states, consequently
causing the notion of an observer to be ill-defined.

– 3 –



J
H
E
P
0
5
(
2
0
2
5
)
0
5
9

corresponding kets. In contrast, if we are interested in global questions that do not depend
on the presence of a bulk observer — e.g. the entropy of Hawking radiation of a subsystem
of the dual holographic theory, boundary correlation functions, etc. — we should treat all
worldlines and matter fields in the same way and use the usual rules for the gravitational
path integral in the absence of an observer. This implies that most results obtained in recent
years using the non-perturbative gravitational path integral remain unchanged.

As we will see, our proposal succeeds in describing non-trivial physics in a closed universe
and in giving new, sensible answers to questions about the experience of observers infalling into
black hole horizons. Furthermore, it shifts the attention away from the global properties of the
spacetime, rather focusing on the non-perturbative physics experienced by a local, gravitating
observer. For these reasons, we believe it represents a new, promising framework for the
description of quantum cosmology and more generally, for the description of spacetimes
without a conventional holographic description.

1.1 Outline and summary of results

In this paper, we focus our attention on two-dimensional Jackiw-Teitelboim (JT) gravity with
a negative cosmological constant [12, 82, 83]. This theory is known to be dual to a random
matrix integral [13]. We will comment on the extension of our results to de Sitter-JT gravity
and higher dimensions in section 7. This paper is structured as follows.

In section 2, we review the relevant properties of AdS-JT gravity (with and without
matter) and the gravitational path integral in the absence of an observer. The results we
obtain in this framework offer a “global picture” for the theory since we do not isolate the
subsystem of the observer in our gravitational theory. In particular, we discuss the dimensions
and properties of the perturbative and non-perturbative quantum gravitational Hilbert spaces
in a closed universe and in a two-sided black hole. Readers familiar with JT gravity can skip to
section 2.3, where we give a new derivation, based on a resolvent calculation, of the fact that
the non-perturbative Hilbert space of closed universes Hnon-pert is one-dimensional [11, 76, 78].

In section 3, we explain our proposal for the modified rules of the gravitational path
integral in the presence of an observer. In our setup, states belong to the tensor product
space Hrel ⊗ Hobs, where states in Hobs describe the observer and states in the relational
Hilbert space Hrel describe the states on the spatial slices of the gravitational theory with
which the observer interacts. We then show how the statistics of overlaps for such states are
modified with the new rules in the gravitational path integral, and consequently define the
perturbative and non-perturbative relational Hilbert spaces, Hrel

pert and Hrel
non-pert, which are

specific instances of Hrel with different choices of inner-product. We discuss various possible
bases of states for these Hilbert spaces, and explain how to define states labeled by the time
read by the observer’s clock, with respect to which observables can be dressed.

In section 4, we compute the dimension of the Hilbert space Hrel
non-pert for a closed universe

and a two-sided black hole,2 using a resolvent calculation [16, 20, 26, 27, 74, 75, 84] and
the new rules for the gravitational path integral. We find that the closed universe Hilbert

2There, we will assume that the gravitational theory is coupled to additional matter sources.
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space is non-trivial and has dimension

dim
(
Hrel

non-pert

)
= d2 as opposed to dim (Hnon-pert) = 1 (1.1)

where d is determined by the density of states in JT gravity and is exponential in G−1
N .

Similarly, the Hilbert space of the two-sided black hole is also larger in the presence of
an observer,

dim
(
Hrel

non-pert

)
= d4 as opposed to dim (Hnon-pert) = d2. (1.2)

Note that the entropy of the observer is bounded above by log
(
dim(Hobs)

)
, and, in particular,

this limits how much information they can learn about the properties of Hrel
non-pert.3

To further characterize the properties of Hrel
non-pert, we show (details can be found in

appendix C) that in both cases, Hrel
non-pert factorises into a tensor product of two Hilbert

spaces that, in two-dimensional gravity, capture the degrees of freedom on the left and right
side of the observer (and two additional Hilbert spaces associated with the left and right
boundaries in the two-sided black hole cases).

In section 5, we show that the inner product defined by our new rules is positive-semi-
definite. Similar to the results of [16, 17, 38], we find that the set of perturbatively-defined
states is an overcomplete basis for Hrel

non-pert. This implies the presence of null states under
the inner product defined by the non-perturbative gravitational path integral. We discuss
these null states and comment on the non-isometric map [85–87] between Hrel

pert and Hrel
non-pert.

Sections 4 and 5 make manifest a puzzling feature of quantum gravity: by isolating a
subsystem — the observer — within the gravitational theory, we consequently restrict the set
of geometries that are included in the gravitational path integral, and actually increase the
dimension of the resulting Hilbert space. This phenomenon is, of course, at the heart of the
Page curve calculations [16, 17, 88, 89], but we are seeing it arise again in the context of the
observer’s Hilbert space, Hrel

non-pert. Importantly, even though one might be tempted to think
that the observer’s Hilbert space can be isolated via a linear projection onto geometries in
which an observer is present, section 4 shows that this cannot be the case; in fact, the Hilbert
space from an observer’s point of view is larger whereas a projection always reduces the
Hilbert space dimension. Furthermore, these results imply that observables that act linearly
(state-independently) on Hrel

non-pert can only be represented non-linearly (state-dependently)
on Hnon-pert [86, 87, 90, 91]. This is in agreement with arguments that the infalling observer’s
experience should not be fully describable by linear operators on Hnon-pert [90–92].

In section 6, we study several examples of observables defined on Hrel
non-pert that are

relevant to probe the experience of a gravitating observer. In the closed universe setup,
we study correlation functions along the observer’s worldline and find that they are non-
trivial. In particular, away from the cosmological singularities, they do not receive large

3To quantify the amount of information that the observer can learn about Hrel
non-pert one can use the

maximum possible von Neumann entropy of the observer among all states within Hrel
non-pert ⊗Hobs. This is

given by min(log dim(Hobs), log dim(Hrel
non-pert)) with dim

(
Hrel

non-pert
)

given in (1.1) for the closed universe
and (1.2) for the two-sided black hole. Nevertheless, choosing different states in Hrel

non-pert⊗Hobs yields different
results for the observables that the observer can measure, and, for this reason, it is valuable to be able to
understand the full relational Hilbert space that is entangled with the observer.
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non-perturbative corrections and, therefore, agree with the perturbative result. This is in
contrast with the global perspective, in which the one-dimensional Hilbert space for the closed
universe implies that all observables are trivially multiples of the identity, and the perturbative
result receives large non-perturbative corrections. We then study several interesting properties
of the perturbative correlators and point out that the structure of their divergences could
be used to probe the cosmological singularity. In the two-sided black hole case, we study
two observables relevant for describing the physics of an infalling observer: the length of the
Einstein-Rosen bridge [37, 38, 71, 93] and the center-of-mass collision energy of an observer
with a shockwave past the horizon [38]. Both of these observables were studied in detail
in [38] in the global picture — namely, as observables on Hnon-pert. For the length, we find
that the result obtained in the global picture is substantially unmodified: non-perturbative
corrections become important at times t = O(eS0), and cause the length to plateau. For
the center-of-mass collision energy, we also find that non-perturbative corrections to the
perturbative result are only important at times t = O(eS0). This is in contrast with recent
puzzling results in the global picture [38] (reviewed in section 6.3), where non-perturbative
effects become important at linear times t = O(S0), suggesting a breakdown of effective field
theory roughly at the Page time. Our result resolves this puzzle and signals that perturbative
effective field theory remains valid up to exponential times, assuming our proposal is correct.

In section 7, we discuss our results, their generalization to higher dimensions, and other
future directions. We discuss the relationship between our proposal and other frameworks
for the description of physics with respect to a gravitating observer. We also consider what
lessons can be drawn from our results for the definition of a holographic dual theory able
to capture the observer’s experience and suggest that such a theory should live on the
worldline of the observer. Finally, we explain how our results can be extended to describe
the experience of an observer in de Sitter spacetime.

Additional technical details relevant to the main sections of this paper can be found
in the appendices.

2 Review: non-perturbative effects in quantum gravity

Non-perturbative corrections to the gravitational path integral have recently proven essential
to the description of many quantum gravity phenomena. Described colloquially as “wormhole
corrections” after the work of [8], these effects have been used to explain the Page curve [16, 17],
factorization [15, 18, 21] and factorisation [74, 94], and black hole microstate counting [16,
17, 20, 22, 26, 27]. In this section, we provide a review of how wormholes can be used to
build a fully non-perturbative Hilbert space for JT gravity with and without matter and
how to compute the dimension of the Hilbert space in a closed universe. As explained
in [11, 76, 78], we find that the Hilbert space of closed universes is far too small to adequately
capture states of interest.

This section adopts and reviews the global perspective of previous literature. For our
proposed modifications to these rules in the presence of an observer, see section 3.

– 6 –
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2.1 The perturbative Hilbert space

We take our theory to be JT gravity [82, 83, 95] with a negative cosmological constant and
matter [38, 96, 97]. This is a 2D theory of a metric g coupled to a dilaton Φ and matter fields
ϕ on a manifold M , possibly with boundary. In Euclidean signature the action takes the form

I[g,Φ, ϕ] = IEH [g] + IΦ[g,Φ] + Im[g, ϕ], (2.1)

where

IEH [g] = −S0χ(M) and IΦ[g,Φ] = −1
2

(∫
M

Φ(R+ 2) + IΦ,∂M [h,Φb]
)
, (2.2)

where χ(M) is the Euler characteristic, h the restriction of g to ∂M , and Φb the value of Φ on
∂M . The boundary dilaton action depends on the theory in question. The action of the matter
fields Im[g, ϕ] is left unspecified except to demand that matter does not directly couple to the
dilaton. We build up the Hilbert space associated with this action by considering each term
separately. First is IEH , the purely gravitational part of the action. This term is a topological
invariant. For now, we take S0 to be a tunable parameter and consider the limit S0 → ∞.
In more general theories of gravity, S0 would be replaced by a dimensionless parameter
scaling with G−1

N , the inverse of Newton’s constant. The resultant quantum mechanics can
be made exact to all orders in loop corrections [98, 99] but will have topological fluctuations
suppressed. We call this the perturbative limit of the theory. In the non-perturbative limit,
we take S0 to be a large but finite parameter.

The leading contribution to the gravitational path integral with action (2.1) has the
topology of a disk. Let us consider the dilaton action with respect to this background,
starting with the two-sided black hole. We set

IΦ,∂M [h,Φb] = 2
∫

∂M
Φb(K − 1), (2.3)

choosing Dirichlet boundary conditions for the dilaton and Neumann boundary conditions
for the extrinsic curvature. We then have

ds2 = hijdx
idxj = 1

ϵ2
dτ2 and Φ|∂M = Φb

ϵ
(2.4)

with τ ∼ τ +β, where β is the renormalized asymptotic boundary length, which remains finite
as we take ϵ→ 0. We also choose units such that Φb = 1. What remains is a two-dimensional
phase space. Semiclassically, these parameters are ℓ, the geodesic length of a Cauchy slice
connecting the left and right boundaries, and its conjugate momentum. Time evolution on
the left and right boundaries are generated by the same ADM Hamiltonian

HL = HR = −1
2∂

2
ℓ + 2e−ℓ. (2.5)

The constraint H0 = HL −HR = 0 is a consequence of the gauged SL(2,R) symmetry. The
resultant Hilbert space is familiar

H0 =
{
|ℓ⟩ ; ℓ ∈ R and

〈
ℓ
∣∣ℓ′〉 = δ(ℓ− ℓ′)

}
= L2(R) (2.6)

and is manifestly the space of gauge invariants H0 |ℓ⟩ = 0.

– 7 –
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We can build generic wavefunctions for any state |ψ⟩ ∈ H0 by taking overlaps

ψ(ℓ) = ⟨ℓ|ψ⟩ and ⟨ψ|ψ⟩ =
∫
dℓ |ψ(ℓ)|2. (2.7)

Let us introduce two other useful spanning sets of H0. The states of either set can be
considered Hartle-Hawking wavefunctions as they represent semiclassical spacetimes with
specific boundary conditions. First is the fixed energy basis4

H0 =
{
|E⟩ =

∣∣∣s ≡ √
2E
〉
; E ∈ R+ and

〈
E
∣∣E′〉 = δ(s− s′)

ρ0(s)

}
(2.8)

defined by wavefunctions

φ̃s(ℓ) ≡ ⟨ℓ|E⟩ = 4K2is(4e−ℓ/2) (2.9)

that diagonalize HL and HR. Here Kα(x) is the modified Bessel function of the second-kind.
The relevant density of states is

ρ0(s) =
s

2π2 sinh(2πs) or ρ0(E) = ρ0(s =
√
2E)√

2E
. (2.10)

Of course, the true density of states is ρ = eS0ρ0. Throughout this paper, we extract factors
of eS0 from the density of states and include them explicitly in our calculations to clarify
which terms are relevant at each order in the genus expansion.

We also consider the set of states {|β⟩ ; β ∈ R+} defined through fixed asymptotic length
boundary conditions in the gravitational path integral

φβ(ℓ) ≡ e−S0/2 ⟨ℓ|β⟩ ≡
∫
dsρ0(s) e−

βs2
2 φ̃s(ℓ) = e−S0 × . (2.11)

The states in this basis are not orthogonal to each other. Their overlaps compute partition
functions

Z(β = β1 + β2) = ⟨β1|β2⟩ = eS0

∫
dsρ0(s) e−

(β1+β2)s2
2 = , (2.12)

for a spacetime of fixed asymptotic length β = β1+β2. Note the need to manually reintroduce
factors of eS0 because of the convention for ρ established above. The diagrammatic notation
in equations (2.11) and (2.12) reflects the fact that the {|ℓ⟩} and {|β⟩} bases are related by
bulk evolution through the path integral. As we will discuss further in section 3, since the

4We use s and E interchangeably throughout. The reader is encouraged to consider s as the momentum
associated with E, but in all cases, we simply have s =

√
2E.
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Wheeler-DeWitt evolution which governs bulk dynamics is pure gauge [100], this amounts to a
change of basis rather than actual dynamics. For future reference we also define Zn(β1, · · · , βn)
as the generalization of Z to a geometry with n-boundaries. At the perturbative level this
is just the product of n-disk partition functions

Zn(β1, · · · , βn) = × · · · × ,

=
n∏

i=1
Z(βi).

(2.13)

Let us now consider the Hilbert space of closed universes. We work with spacetimes
whose spatial slices are compact [7, 11, 76]. Setting

IΦ,∂M [h,Φb] = 0 (2.14)

gives closed Big Bang-Big Crunch cosmologies in Lorentzian signature. In Euclidean signature,
this leads to wormholes connecting two asymptotic AdS boundaries, as shown in figure 2.
Again, the phase space is two-dimensional. The Hilbert space is spanned by states of the form

H0 =

|b⟩ ; b ∈ R+ and
〈
b
∣∣b′〉 ≡ = 1

b
δ(b− b′)

 (2.15)

where b is the length of the maximal slice of the closed universe in Lorentzian signature
(or, equivalently, of the minimal slice of the wormhole in Euclidean signature). This slice is
depicted in dark blue in figure 2. The diagrammatic notation captures that the inner product
for closed universes is defined through the path integral. We can also define states of fixed
asymptotic boundary length in Euclidean signature through the path integral

φβ(b) = ⟨b|β⟩ = . (2.16)

In the absence of matter, such wavefunctions are dominated by vanishingly small values of b.
So far, we have analyzed pure JT gravity. Now we add matter starting with the two-sided

black hole as the background. Semiclassically, we quantize the matter fields on a Cauchy
slice of fixed length ℓ. These fields come in representations of the background spacetime
isometries, which in this case are given by the group SL(2,R). For now, we will suppress
internal matter degrees of freedom such that it suffices to consider

Hm = C⊕
⊕
∆

D+
∆. (2.17)

– 9 –
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Figure 2. (Left) A Lorentzian Big Bang-Big Crunch closed universe with a Cauchy slice of maximal
length b (depicted in blue). (Right) Its Euclidean counterpart has two AdS asymptotic boundaries
connected by a Euclidean wormhole. The geodesic slice of minimal length b is identical to the maximal
slice in Lorentzian signature. This length is vanishingly small on-shell when the wormhole is not
supported by matter and is finite in the presence of matter.

Here C refers to the trivial representation of SL(2,R) and each D+
∆ corresponds to the block

descendant from a “primary” operator O∆ of scaling dimension ∆ living on the boundary.5

We ignore the trivial representation throughout this work. Let H , P , and B be the generators
of global time translations, spatial translations, and boosts in SL(2,R).6 The Casimir
determining the representation is

C∆ = H2 − P 2 −B2 = ∆(∆− 1). (2.18)

Alternatively, ∆ is the smallest H eigenvalue in D+
∆. We choose the lowest weight represen-

tation so that the total energy is bounded from below.
Let us label different states in a representation D+

∆ by an integer m corresponding to
their H eigenvalue. Since the dilaton does not interact with the matter sector, the new
Hilbert space is just a tensor product

Hpert = Hm ⊗H0 = {|∆; ℓ,m⟩ ;
〈
∆; ℓ,m

∣∣∆′; ℓ′,m′〉 = δ∆,∆′δ(ℓ− ℓ′)δm,m′}. (2.19)

The constraints are also changed by the presence of matter. For one thing, it is no longer true
that the difference of boundary ADM Hamiltonians annihilates physical states. Instead [38]

HL = 1
2

(
−i∂ℓ +

1
2P
)2

+ (H −B)e−ℓ/2 + 2e−ℓ,

HR = 1
2

(
−i∂ℓ −

1
2P
)2

+ (H +B)e−ℓ/2 + 2e−ℓ,

(2.20)

and the new SL(2,R) constraints depend on the action of the symmetries on the matter fields.
One way to implement these constraints is to construct Hpert as the space of co-invariants
drawn from the tensor product of Hm and the unconstrained pure JT Hilbert space [96, 101].

5A representation theorist would call ∆ a weight and D+
∆ the set of roots descendant from this weight.

To a quantum mechanic, D+
∆ is simply the set of states with some total angular moment ∆. Today, we are

geometers.
6In terms of angular momentum operators, we have

H = iLz P = L− − L+

2 B = iL− − iL+

2 .
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It turns out that we can rewrite [97]

Hpert = L2(R+)0 ⊕
⊕
∆
L2(R+)L ⊗ L2(R+)R. (2.21)

The first L2(R+)0 is the vacuum sector of the theory where we have no matter insertions. It
is precisely H0 when states are labeled by their energies. We’ll be ignoring this sector so that
we can focus our attention on the quantum matter. The left and right Hamiltonians defined
above give a complete set of mutually commuting operators in a given representation

[C,HL] = [C,HR] = [HL, HR] = 0. (2.22)

The direct sum is over representations where L2(R+)L and L2(R+)R refer to the energy on
the left and right boundaries, respectively. In analogy with the vacuum sector, we label
these states as

Hpert =
{
|∆;EL, ER⟩ =

∣∣∣∆; sL ≡
√
2EL, sR ≡

√
2ER

〉
;

〈
∆;EL, ER

∣∣∆′;E′
L, E

′
R

〉
= δ∆,∆′

δ(EL − E′
L)

ρ0(EL)
δ(ER − E′

R)
ρ0(ER)

γ∆(EL, ER)
} (2.23)

where the Hilbert space is defined up to a choice of normalization γ∆ for our states. We
choose the normalization such that overlaps calculate physically meaningful observables

γ∆(EL, ER) =
∏
±,±

Γ(∆± i
√
2EL ± i

√
2ER)

22∆−1Γ(2∆) = ⟨EL|e−∆ℓ|ER⟩ . (2.24)

In the first equality, we take a product over the four choices of ±, and in the second, we
calculate the overlap in H0. We define a ∆-sector specific wavefunction φ̃∆

EL,ER
(ℓ,m) to act

as the change-of-basis metric between our two representations of Hpert

|∆;EL, ER⟩ =
∑∫
m

dℓ φ̃∆
EL,ER

(ℓ,m) |∆; ℓ,m⟩ . (2.25)

As in the case without matter, we can define a non-orthogonal set of Laplace conju-
gate states

|∆;βL, βR⟩ = eS0/2
∫
dsLdsRρ0(sL)ρ0(sR) e−

βLs2
L

2 −
βRs2

R
2 |∆; sL, sR⟩ . (2.26)

With our choice of normalization, overlaps compute thermal two-point functions [95]. That is

〈
∆i;β(1)L , β

(1)
R

∣∣∣∆j ;β(2)L , β
(2)
R

〉
= δ∆i,∆j

= δ∆i,∆j
eS0

∫
dsLdsRρ0(sL)ρ0(sR)e−

βLs2
L

2 e−
βRs2

R
2 γ∆(sL, sR).

(2.27)
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where βL = β
(1)
L + β

(2)
L and βR = β

(1)
R + β

(2)
R . Alternatively, we can define〈

∆i;β(1)L , β
(1)
R

∣∣∣∆j ;β(2)L , β
(2)
R

〉
= δ∆i,∆j

⟨O∆|e−βLHL−βRHR |O∆⟩ (2.28)

where |O∆⟩ = |∆;βL = βR = 0⟩ is prepared by acting on the maximally entangled state with
a primary O∆.7 We can generalize the n-boundary partition function to the inclusion of
matter. This is a multi-trace operator in the sense of [13]

Z
i1,i′1,··· ,in,i′n
n (β1,L, β1,R, · · · , βn,L, βn,R)

= δ∆i1 ,∆i′1
× · · · × δ∆in ,∆i′n

,

=
n∏

k=1

[
δ∆ik

,∆i′
k

eS0

∫
dsLdsRρ0(sL)ρ0(sR)e−

βk,Ls2
L

2 e−
βk,Rs2

R
2 γ∆ik

(sL, sR)
]
.

(2.29)

The superscripts indicate the matter flavor indices i1, i′1, · · · , in, i′n and βk,L, βk,R are the
total left and right boundary lengths for each overlap. Here, we associate the flavor indices
ik with different scaling dimensions ∆ik

of the matter operators, but they could alternatively
be associated with an internal symmetry of the matter sector. We choose matter fields whose
one-point function vanishes so that we are forced to contract matter indices in all diagrams.
Again, at the perturbative level, this is just the product of single-trace operators.

The analysis proceeds similarly for closed universes. We start by including matter
insertions in the preparation of the state of the closed universe. Like the two-sided black
hole, the new Hilbert space is a tensor product

Hpert = Hm ⊗H0 =


|∆;β⟩ ;

〈
∆;β

∣∣∆′;β′
〉
= δ∆,∆′


(2.30)

where, again, the inner product is defined through the path integral. Closed universe states
can be labeled by a matter scaling dimension ∆ and the asymptotic length of the boundary
β. These states are normalized such that their overlaps compute the double-trace operator

⟨∆;β|∆;β⟩ = (Tre−βHO∆)2, (2.31)

where H generates asymptotic boundary time evolution. Unlike pure JT gravity, the Euclidean
wormholes associated with closed universes are stabilized in the presence of matter, and
wavefunctions are dominated by finite values of b [76]. We discuss how these states can be
represented on more general Cauchy slices (other than asymptotic boundaries) in section 3.

7This state is not normalizable unless we restrict ourselves to a finite energy window. States of this form
will be useful when defining inner products in matrix theory, and we revisit them in section 5.
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We can explicitly compute these overlaps by slicing the path integrals open along the
matter insertion. With fixed energy boundary conditions, a geodesic worldline ending on
the insertion of a dimension ∆ matter operator contributes a factor e−∆ℓ/2φ̃s(ℓ) to the path
integral. We consider

〈
∆;β′

∣∣∆;β
〉
=
∫
dℓe−∆ℓ

=
∫
dsρ0(s)dℓe−∆ℓ φ̃s(ℓ)e−βs2/2φ̃s(ℓ)e−β′s2/2,

(2.32)

where we have treated the exponential factors as a modification to the ℓ-measure. In the first
line, we cut open the path integral of equation (2.31) along the matter geodesic, and, in the
second line, we reinterpreted the resulting diagram as an integral. We could alternatively
depict the integral as a trace over the energy to emphasize how the boundary conditions
form a closed cycle. This rewriting is conducive to the dual matrix integral [13, 102] where
the parameter s is replaced by a random matrix. We discuss the semiclassical interpretation
of the matrix model below.

2.2 Non-perturbative effects

The perturbative Hilbert spaces we have discussed so far are infinite-dimensional. To see
how this might change in the non-perturbative case, we consider an analogy inspired by [86].
Suppose we are given a set of unit vectors {|vi⟩}K

i=1 randomly pulled from an inner product
space Hnon-pert. The span of these vectors determines a new Hilbert space H(K) with inner
product inherited from Hnon-pert. We are tasked with uncovering the size of Hnon-pert by
conducting experiments in H(K). If dim(Hnon-pert) ≫ 1 then any two vectors are very
likely orthogonal. That is

⟨vi|vj⟩ = δij . (2.33)

The overline · denotes expectation values taken over many realizations of H(K). We can
quantify how clearly this expectation captures the underlying vector space statistics by
considering higher-order moments. The second moment is

|⟨vi|vj⟩|2 = δij +O

( 1
dim(H(K))

)
(2.34)

which means that the variance roughly computes the size of the Hilbert space

σ2 = |⟨vi|vj⟩|2 −
∣∣∣⟨vi|vj⟩

∣∣∣2 = O

( 1
dim(H(K))

)
. (2.35)

This implies that we should not always expect to find dim(H(K)) = K. Instead, dim(H(K))
saturates as K approaches dim(Hnon-pert) and the likelihood of encountering linear dependence
between two vectors approaches O(1).
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Non-perturbative quantum gravity produces a situation quite analogous to the toy model
above. Let us focus our attention on an arbitrary but finite energy window. Quantum field
theory on a fixed background teaches us to expect infinite-dimensional Hilbert spaces. This is
the perturbative quantum gravity limit introduced in the previous section. Non-perturbative
quantum gravity confounds this expectation by assigning a large but finite entropy S0 to
regions of spacetime. A basis in the perturbative Hilbert space must become overcomplete
in the finite, non-perturbative Hilbert space.8 We have not yet developed the technology to
compute exact overlaps in the non-perturbative Hilbert space of quantum gravity Hnon-pert.9

But in the specific case of JT gravity, non-perturbative wormhole effects can be captured by
the random matrix integral of [13]. Accordingly, wormhole corrections to overlaps computed
using the gravitational path integral capture the statistical fluctuations of the inner product,
viewed as a random variable drawn from the matrix ensemble [11–15, 25, 103].

Let us consider some examples of wormhole corrections in the two-sided black hole case.
Non-perturbative effects modify the inner product:10

⟨ℓ|ℓ′⟩ = δ(ℓ− ℓ′) + +O(e−4S0),

⟨b|b′⟩ = 1
b
δ(b− b′) + +O(e−4S0)

(2.36)

Moving forward, we exclusively use the overline · to denote expectation values computed using
the full gravitational path integral. We can also consider how non-perturbative effects modify
Zn. While the leading order term is still the product of n-disks given in equation (2.13),
we also pick up connected terms like

Zn(β1, · · · , βn) ⊃ e(2−n)S0




(2.37)

where ⊃ is used to denote summands in the genus expansion. These new terms are especially
important after the inclusion of matter. The leading perturbative term in Z

i1,i′1,··· ,in,i′n
n

8We make a technical distinction between H and Hpert. Since states in either space can be determined by
analogous boundary conditions, we employ a slight abuse of notation and use identical labels for the states in
either space, but the inner products on these spaces are distinct, so they are not equivalent as Hilbert spaces.
In reality, there is a non-isometric map V : Hpert → Hnon-pert that lets us elevate a subset H ⊂ Hpert to a
subspace V (H) ⊂ Hnon-pert. This section studies how the kernel of this map grows as a function of K.

9A notable exception is AdS/CFT, where overlaps in quantum gravity are given by well-understood overlaps
in a dual CFT.

10One might hope that these effects are small enough that the states in the set {|ℓ⟩} are still all linearly
independent in Hnon-pert. We will soon see that this is not true. The states span the full Hilbert space, but
now the set is overcomplete. We explicitly discuss linear dependence and the emergence of null states in
section 5.
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appears with a product of δ-functions. If ik ̸= i′k in equation (2.29), then the leading bulk
geometry must connect the k-th boundary to a disjoint boundary. If we contract the indices
cyclically and ik ̸= i′k ∀k, then the leading contribution to the non-perturbative calculation
is a fully connected geometry

Zi1,i2,i2,··· ,in,i1
n (β1,L, β1,R, · · · , βn,L, βn,R) ⊃ e(2−n)S0




,

= e2S0

∫
dsLdsRρ0(sL)ρ0(sR)

n∏
k=1

yk(sL, sR)

(2.38)

where
yk(sL, sR) = e−S0e−

βk,Ls2
L

2 e−
βk,Rs2

R
2 γ∆ik

(sL, sR). (2.39)

Moving forward, we’ll refer to this path integral as the pinwheel geometry [74]. It is
computed by noting that the geometry is made of two connected components separated by
matter worldlines. These components are glued along the matter lines by the two energy
integrals. The yk factors carry the contribution from the k-th boundary to the path integral.
This consists of a factor of e−S0 needed to compute the Euler characteristic, factors of
e−

βs2
2 = e−βE which specify the boundary length on either end of the matter insertion,

and the normalization factor γ∆ introduced in equation (2.24). The pinwheel is dominant
for a cyclic index contraction as long as matter indices on the same boundary differ (i.e.,
ik ̸= i′k ∀k). Otherwise, the leading contribution is the disconnected diagram given in
equation (2.29). In the perturbative limit S0 → ∞, all of these corrections vanish, and we
recoup equations (2.6), (2.13), and (2.29).

Equation (2.35) gives us a way to estimate the size of the Hilbert space, but we can
do better. Considering contributions from higher-order moments allows us to find an exact
answer. This can be done systematically by introducing the resolvent [16, 26, 74]

Rij(λ) ≡
( 1
λ1−M

)
ij
,

= δij

λ
+ 1
λ

∞∑
n=1

(Mn)ij

λn
,

(2.40)

where M is the Gram matrix

Mij ≡ ⟨vi|vj⟩ (2.41)

and λ ∈ C. The number of non-zero eigenvalues of the Gram matrix counts the dimen-
sion of the Hilbert space spanned by the set {|vi⟩}, i = 1, . . . ,K. Roughly speaking, an
eigenvalue z of M manifests as a non-analyticity on Rij with multiplicity given by the
residue Resλ=z(

∑
iRii(λ)). Integrating R on a contour which excludes λ = 0 and no other

eigenvalues counts the dimension of H(K) = Span({|vi⟩}). If we also compute powers of
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Figure 3. The integration contour needed to calculate the Hilbert space dimension consists of the
large defining contour of the resolvent C∞ and a small contour C0 used to exclude the contributions
from zero eigenvalues of the Gram matrix.

the Gram matrix using the gravitational path integral, we get an expectation value for
dim(H(K)) as a subset of the non-perturbative Hilbert space H(K) ⊂ Hnon-pert. We review
the analytic structure of the resolvent and how to arrive at this result from a replica trick
in appendix A. In summary, we have

dim(H(K)) =
∮

C

dλ

2πiR(λ) (2.42)

where the contour C = C0 ⊔ C∞ is defined in figure 3 and R =
∑

iRii is the trace of
the resolvent.11

In appendix B, we use equation (2.42) to find the size of a K-dimensional subspace of
the perturbative Hilbert space of two-sided black holes under the non-perturbative inner
product. In the double-scaling limit K → ∞, e2S0 → ∞ with K/e2S0 = O(1), we find

dim(Hnon-pert(K)) =

K K < d2,

d2 K > d2,
(2.43)

where
d ≡ eS0

∫
dEρ0(E) (2.44)

is given by an integral over an arbitrary but finite energy window. We reintroduced here
the energy variable E = s2/2, with the relationship between ρ0(E) and ρ0(s) given in
equation (2.10). Since this result is basis-independent, we conclude that the non-perturbative
Hilbert space for an arbitrary but finite energy window has dimension dim(Hnon-pert) = d2.

2.3 The Hilbert space of closed universes

Our goal in this section is to derive the dimension of the non-perturbative Hilbert space of
closed universes. For simplicity, we consider a fixed scaling dimension ∆ and asymptotic

11Based on our earlier convention, we should really be referring to R(λ). We hope the reader will allow us
this conceit to slightly unburden the notation moving forward.
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length β. States are only differentiated by an internal flavor index i

Hnon-pert(K) = Span {|qi⟩ ; i ∈ {1, · · · ,K}} . (2.45)

We establish these conventions strictly for computational convenience.12 We will show that
this choice has no effect on our final result by proving that the {|qi⟩} states are overcomplete
in Hnon-pert if we take K sufficiently large [16, 17, 20, 26, 27].

The non-perturbative inner product is given by the topological expansion

⟨qi|qj⟩ = = δij


+O(e−2S0)


(2.46)

Note how the leading geometry appears at O(1) when expanding in powers of eS0 . The
Kronecker delta ensures that lines that connect to each other carry the same flavor index.
The second moment of this overlap looks like

| ⟨qi|qj⟩ |2=

= δij


+


+ +O(e−2S0).

(2.47)

Equations (2.46) and (2.47) imply that the variance of the overlap is also O(1) in powers of
eS0 . By equation (3.7), we can then estimate dim(Hnon-pert) = O(1). Like with the two-sided
black hole, we see that the non-perturbative inner product greatly reduces the dimension
of the Hilbert space. However, in this case, it seems as though there are very few states.
This could not be true for the two-sided black hole because we could produce physically
inequivalent states by evolving with the boundary ADM Hamiltonians HL and HR. We
have no such option here, and our result implies that trivial bulk “evolution” generated
by the Wheeler-DeWitt Hamiltonian is enough to span the Hilbert space. In other words,
all bulk degrees of freedom are gauge.

12For example, one could alternatively define

Hnon-pert(K) = {|qi⟩ = |∆i;β⟩ ; i ∈ {1, · · · k} and ∆i ≈ ∆}

for similar constants ∆ and β or consider states labeled by different values of β. These sets are linearly
independent from each other in the perturbative Hilbert space Hpert, but span the same space in Hnon-pert.
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To move past order-of-magnitude estimates, we need to include contributions from all
moments as prescribed by equation (2.42). As a first step, let us compute the resolvent
Rij , defined in equation (2.40), using the gravitational path integral. For closed universes,
each power of the Gram matrix M necessitates the inclusion of two disconnected boundaries.
For a given power (Mn)ij , matter indices are assigned cyclically and summed over for all
but two adjacent boundaries13

= + + + · · ·

= + +



+

+



+ · · ·

(2.48)

The leading geometries are not fully connected. In the black hole case (cf. appendix B),
the pinwheel geometry allowed us to contract like indices at the cost of a higher Euler
characteristic. Here, each matter insertion lives on a distinct boundary, meaning that we can
form index loops without ever needing to connect more than two boundaries. We drop terms
which are exponentially suppressed in S0 so that the resolvent is fully calculable in powers of

Zclosed
1 =

∫
dsρ0(s) e−βs2γ∆(s, s) = (2.49)

Note that while Zclosed
1 is topologically identical to Z2 introduced in equation (2.38), it has

half as many matter insertions.

13Here, we explain the notation used in the diagrammatic expansion. Blue and green lines carry an index.
Blue lines are “bare propagators”. Green lines denote bulk matter. The intersection of any two lines comes
with a Kronecker delta, which imposes that they both carry the same index. Internal indices are summed over.
In particular, we sum over the index in all loops. Blue lines not contracted with the insertion of a resolvent
come with a factor of 1/λ.
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In the double scaling limit e2S0 → ∞, K → ∞ with K/e2S0 = O(1), at leading order
in K we get a single summand from each power TrMn where n copies of Zclosed

1 are used
to connect like indices

= + + + · · ·

(2.50)

After taking the trace on both sides, in equation form we have

λR(λ) = K +
∞∑

n=1

(
KZclosed

1
λ

)n

,

= K + KZclosed
1

λ−KZclosed
1

.

(2.51)

The resolvent has a single non-zero pole at λ = KZclosed
1 . Plugging into equation (2.42)

gives precisely dim(Hnon-pert(K)) = 1.
Before concluding that the Hilbert space is trivial, we should check how subleading

corrections in K affect our answer when we move away from the K → ∞ limit. Our approach
is recursive. We start with the fact that TrM = KZclosed

1 at leading order in eS0 . Now
suppose that we know TrMn−1 and want to calculate

TrMn = (Mn−1)i1,in(M)in,i1 (2.52)

where repeated indices are summed over. The simplest contributions to the trace come
from diagrams where the in indices are contracted together through Zclosed

1 . Such diagrams
contribute as

TrMn ⊃ TrMn−1 · TrM = KZclosed
1 TrMn−1. (2.53)

Only considering such terms would yield the approximation studied above, but in general we
can contract one of the in indices with any of the 2(n−1) other ik indices. These contractions
give factors of δik,inZ

closed
1 . We spend the delta by swapping the remaining in index for an

ik leaving another copy of TrMn−1

TrMn ⊃ Zclosed
1 (Mk−2)i1,ik−1Mik−1,inMin,ik+1(M

n−k−2)ik+1,in−1Min−1,i1

= Zclosed
1 TrMn−1.

(2.54)
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In total we have

TrMn = Zclosed
1 (K + 2(n− 1))TrMn−1 =

(
2Zclosed

1

)n
(
K

2

)(n)
(2.55)

where x(n) = Γ(x+n)
Γ(x) is the Pochhammer symbol.14

We can now present a formula for the resolvent that is valid for any K. After taking
the trace on both sides, equation (2.40) becomes

λR(λ)−K =
∞∑

n=1

(
2Zclosed

1
λ

)n (
K

2

)(n)
,

= 1
Γ
(

K
2

)∑∫ dt

(
2tZclosed

1
λ

)n

tK/2−1e−t,

= 1
Γ
(

K
2

) ∫ dt
2tK/2Zclosed

1 e−t

λ− 2tZclosed
1

.

(2.56)

The right hand side has poles on the entire real axis so we need a slightly different contour to
evaluate equation (2.42). We calculate the principle value for a set of concentric contours
Cϵ
+ wrapping (ϵ,∞) ⊂ R+. This gives

dim(Hnon-pert(K)) = lim
ϵ→0

1
Γ
(

K
2

) ∫ ∞

0
dt 2tK/2Zclosed

1 e−t
∮

Cϵ
+

dλ

2πi
1

λ
(
λ− 2tZclosed

1
) ,

= lim
ϵ→0

1
Γ
(

K
2

) ∫ ∞

ϵ
dt tK/2−1e−t = 1,

(2.57)

where the last line follows from the definition of the Gamma function. Since Hnon-pert(K)
remains trivial for all values of K we can now be certain that there is only one state in Hnon-pert.

3 Setup: the path integral from an observer’s point of view

In section 2, we found that, if we treat all operator insertions on the boundary in the same
way, the gravitational path integral gives a non-perturbative Hilbert space of a closed universe
that is one-dimensional and a non-perturbative Hilbert space of a two-sided black hole that
has dimension d2. As we pointed out in section 1, this result is unsatisfactory if we are

14The authors of [76] computed TrM using an integral over α-sectors. Our result can be rewritten as

TrMn = 1
Γ
(

k
2

) ∫ dt (2Zclosed
1 )ntK/2+n−1e−t

which, after substituting t = x/2, gives

TrMn = (Zclosed
1 )n ⟨xn⟩

with expectation values computed using

p(x) = xK/2−1e−x/2

2K/2Γ
(

K
2

)
as defined in equation (3.17) of [76].
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interested in the experience of a bulk observer. In fact, the inner product between states with
and without an observer have fluctuations — which contribute at leading order in the closed
universe case — meaning that the notion of a fixed observer is not well-defined. Moreover,
a local observer in a closed universe should experience non-trivial physics, which requires
access to a Hilbert space with dimension much larger than one.

Our goal in this section is to introduce a modification to the rules of the gravitational
path integral, which takes into account the presence of a bulk observer. To simplify the
problem as much as possible, we will model the observer as a localized quantum mechanical
system that propagates through the spacetime. Thus, the observer will travel along a bulk
worldline starting and ending at the location where the observer is created in the states that
we shall prepare using the gravitational path integral. Following the work of [66–68, 70], we
take the action of the observer along this worldline to be given by

Iobserver =
∫
dτ [P∂τQ−Q

√
gττ ] , (3.1)

where Q is the Hamiltonian of the quantum system representing the observer, P is its
canonical conjugate, and gττ is the induced metric along the worldline of the observer, which
is parametrized by τ . The Hilbert space of the observer Hobs is spanned by eigenstates
of Q, whose eigenergies, E(i)

O , are taken to be bounded from below and contained within
some narrow range so that we can approximate E(i)

O ∼ EO. We can label a basis of energy
eigenstates of the observer by

∣∣∣∆(i)
O

〉
∈ Hobs, where ∆(i)

O ∼ ∆O are the AdS scaling dimensions

associated to the energies E(i)
O contained within the narrow window. The observer can build

a clock from the energy levels ∆(i)
O , as long as these energy levels are sufficiently dense.15 We

will sometimes dress observables to the time measured by this clock, in which case we will
assume that the states of the clock showing different times are roughly orthogonal.

In this setup, states prepared by the gravitational path integral live in a tensor prod-
uct space

|ψgrav, ψobs⟩ ∈ Hrel ⊗Hobs (3.2)

where |ψgrav⟩ specifies the state of the metric and matter fields on a given slice subject to the
boundary conditions at the worldline of the observer, which in turn depend on the scaling
dimension ∆(i)

O of the observer. The state of the observer |ψobs⟩ lives in Span({
∣∣∣∆(i)

O

〉
}).

For example, in the two-sided black hole setup at the perturbative level, we could take
|ψgrav, ψobs⟩ =

∣∣∣∆(i)
O ; ℓ,m

〉
⊗
∣∣∣∆(i)

O

〉
. To make sense of the Hilbert space that such states

belong to, we have to specify a positive definite inner product. As in section 2, we will always
compute the inner-product between two such states using the gravitational path integral.

To compute the inner-product ⟨ϕgrav, ϕobs|ψgrav, ψobs⟩ at a perturbative level, one finds the
leading gravitational saddle that interpolates between two spatial slices, one where the state
of the observer is ψobs and other field data is specified by ψgrav, and one where the state of the
observer is ϕobs and other field data is specified by ϕgrav. The inner-product is then computed
by a perturbative expansion of the on-shell action around such a saddle. We will refer to the
Hilbert space that results from this choice of inner-product as Hrel

pert ⊗Hobs where we must
impose the constraint that the energy ∆(i)

O of the observer is the same in Hrel
pert and Hobs.

15The clock can in principle provide an accurate estimate of time for proper times along the worldline of the
clock that are much shorter than the inverse of the typical spacing between neighboring energy levels.
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We are interested in computing observables with respect to a given observer at a non-
perturbative level. We, therefore, want to avoid large overlaps between states in which an
observer is present and states in which it is not, and we want the observer to exist on any
spatial slice in between a given bra and the corresponding ket when computing an overlap
between any two states or moments of an overlap. We achieve this by imposing that the
observer’s worldline must connect the points at which it is inserted in the preparation of
any given bra and the corresponding ket. This guarantees that we can ask questions about
the state of the observer on a given spatial slice or the state of the spatial slice given the
state of the observer. In practice, this new prescription is equivalent to introducing an
additional boundary at the location of the worldline of the observer and then integrating over
all possible geometries in which the worldline of the observer can be included (see figure 1).
The observer’s worldline is allowed to fluctuate between the two points where the observer is
inserted in the bra and ket, and we sum over all worldlines that are topologically inequivalent.
However, we also need to quotient by the mapping class group in the gravitation path integral.
We will often perform this quotient by only considering non-winding geodesics.

We now present a simple example that helps motivate this modification to the usual
rules of path integration. Suppose we would like to calculate the probability of transitioning
from a tensor product state |ψ⟩ describing the system and observer to a state |ϕ⟩. Such a
state |ϕ⟩ could, for instance, be an eigenstate of an operator that the observer is trying to
measure, given that the observer is in a certain state. As an example, they could measure the
stress-tensor that they see along their worldline when their clock reads a given time. This
probability is captured by the expectation value of a projector Πϕ on state |ϕ⟩. In the path
integral, both |ψ⟩ and |ϕ⟩ states are defined by boundary conditions. The probability of the
observer transitioning to a state |ϕ⟩ is given by the probability amplitude squared

p(ϕ) = | ⟨ϕ|ψ⟩ |2 = ⟨ψ|Πϕ|ψ⟩ = , (3.3)

which is a path integral with four boundaries. The straight boundaries fix boundary conditions
for the fields and metric to be in the state |ψ⟩ while the curved boundaries have the fields and
metric in state |ϕ⟩. The red dots stand for observer insertions and can be contracted against
each other through a bulk worldline. The conventional rules of gravity tell us to consider the
contributions of all saddles which satisfy the boundary conditions. Naively this gives

p(ϕ) = + +

︸ ︷︷ ︸
Problematic contribution

+ · · · ,

(3.4)
where the · · · denotes other possible contributions to the GPI that we drop for simplicity.
The third contribution above does not compute the probability that the bulk and observer
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are in a given state because the slice on which the projector is inserted never intersects the
worldline of the observer whose state is prepared by the boundary conditions fixed by |ψ⟩.
In fact, the projector inserts a copy of the observer in ⟨ϕ|, which is then measured in |ϕ⟩.
This observer has nothing to do with the one inserted in |ψ⟩ and is simply a consequence
of the insertion of the projector.

As an example, let us consider the states of a closed universe when an observer is present.
With the conventional rules of the gravitational path integral,

p(ϕ) = = + +

︸ ︷︷ ︸
Problematic contributions

(3.5)

at leading order. Similar to the more general example above, the last two contributions
do not compute a transition probability for the state of the system and observer from the
initial state |ψ⟩ to the desired state |ϕ⟩. In the second contribution, the observer connects
cyclically within the projector, and the diagram simply computes the product of the norms of
the two states |ψ⟩ and |ϕ⟩. The third contribution showcases contractions between kets and
bras, which are irrelevant for computing a transition probability. In both cases, the observer
never encounters the slice where the measurement takes place. Our proposed rules for the
gravitational path integral in the presence of an observer, in which an observer created in a
given ket must be annihilated in the corresponding ket, naturally exclude the last contribution
in equation (3.4) as well as the second and third contributions in equation (3.5), leading to
the correct transition probability for the observer and system.

We will call the Hilbert space that results from this choice of inner-product at the path
integral level as Hrel

non-pert ⊗Hobs. Here, Hrel
non-pert is defined as the quantum gravity Hilbert

space on which the operators that are relevant to describe the experience of any observer act
linearly. We will find that at the non-perturbative level (see section 5), states in Hrel

non-pert

are not labeled by the observer’s energy ∆(i)
O which labels states in Hobs. In particular, this

implies that the dimension of the full Hilbert space is dim(Hrel
non-pert)× dim(Hobs) and that

dim(Hrel
non-pert) is independent of the size of the observer’s Hilbert space Hobs (see section 4).

However, the amount of information a given observer can learn about the entire system
is bounded by the von-Neumann entropy of the observer. The maximum value of this
entropy is min(dim(Hobs), dim(Hrel

non-pert)) — which is dim(Hobs) if the dimension of the
observer’s Hilbert space is smaller than that of the rest of the system and dim(Hrel

non-pert)
if, in likely unrealistic models, the dimension of the observer Hilbert space is greater than
that of the rest of system.

We saw in section 2.3 for the case of closed universes,16 that allowing the worldlines
associated with boundary operator insertions to connect between arbitrary bras and kets leads
to a drastic reduction in the dimension of the Hilbert spaces, from that of the perturbative
Hilbert space Hpert to that of the non-perturbative Hilbert space Hnon-pert. This leads us to

16And in appendix B for the case of two-sided black holes.
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expect that our modification of the inner product described above will further modify this
result, leading to differences in the properties of Hnon-pert, Hrel

pert, and Hrel
non-pert. To emphasize

the drastic differences among these Hilbert spaces (for which the states in the gravitational
path integral are defined by the same boundary conditions), we start by analyzing how
moments of overlaps between closed universe states are modified by the new rules. For
simplicity, to start, in this section, we will focus on pure JT gravity in the presence of an
observer without any other matter insertions.

Moments of an overlap in the presence of an observer. We consider asymptotic
states of a closed universe |β,∆(i)

O ⟩ labeled by the length β of the asymptotic boundary
and the scaling dimension ∆(i)

O of the operator insertion associated with the observer. We
will discuss alternative choices of basis states later in this section. As shown in figure 1(a),
an overlap of the form〈

β′,∆(i)
O

∣∣∣β,∆(j)
O

〉
= δij

∫
dEρ0(E)γ∆(E,E)e−(β+β′)E +O(e−2S0) (3.6)

is unchanged because there is only one boundary associated with the bra and one associ-
ated with the ket. The observer’s worldline connects insertions of O(i)

O in the bra to the
corresponding ket regardless of whether we use the old or new rules for the gravitational
path integral. The first significant change comes when computing the square of the overlap
|⟨β′,∆(i)

O |β,∆(j)
O ⟩|2, see figure 1(b). The leading, disconnected geometry is given by a product

of two cylinders, which is simply the square of equation (3.6). The subleading contribution
is given by the genus-zero wormhole depicted on the right of figure 1(b), which computes
the variance of the overlap. This is given by

∣∣∣〈β′,∆(i)
O

∣∣∣β,∆(j)
O

〉∣∣∣2 − ∣∣∣∣〈β′,∆(i)
O

∣∣∣β,∆(j)
O

〉∣∣∣∣2
= e−2S0δij

∫
dEρ(E)ρ(E′)conn.γ∆O

(E,E)γ∆O
(E′, E′)e−(β+β′)(E+E′) +O(e−4S0), (3.7)

where ρ(E)ρ(E′)conn. is given by [13, 104]17

ρ(E)ρ(E′)conn. = − 1
(2π)2

E1 + E2√
E1E2 (E1 − E2)2

. (3.8)

This result is different from what we obtained in section 2.3 using the old rules for the
gravitational path integral. In fact, if we allow the observer’s worldline to connect between
any bra/ket and any other bra/ket, the variance of the overlap is computed by the last two
disconnected geometries depicted in equation (2.47) and is O(1). This implies that the inner
product receives corrections at leading order in the absence of an observer. This fact was
the key mechanism that led to a one-dimensional Hilbert space for the closed universe in
section 2.3. With our new rules, the variance of the overlap (3.7) is O(e−2S0) instead. This
suggests that the dimension of the non-perturbative quantum gravity relational Hilbert space

17Notice that the connected correlator is between the full densities of states ρ(s) = eS0ρ0(s), and the
connected part of the correlator is O(1) [13, 104]. This is why there is an additional factor of e−2S0 in front
of (3.7).
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Figure 4. Overlap between an asymptotic closed universe state |β,∆(i)
O ⟩ and a state defined on the

closed minimal geodesic (depicted in green) |b,∆(i)
O , u⟩. Left: the overlap on the Euclidean cylinder.

The state on the minimal closed geodesic is labeled by the length b of the closed minimal geodesic and
the length u of a geodesic segment wrapping the cylinder once and intersecting the observer’s worldline
perpendicularly at both ends. Right: the cylinder can be cut along the observer’s worldline and
embedded in the Poincaré disk (depicted in black), with the two red lines identified. The contribution
of this geometry to the path integral can be decomposed into a Hartle-Hawking wavefunction ϕβ(ℓi),
with ℓi the length of a geodesic starting and ending at the insertion of the observer on the asymptotic
boundary, and a quadrilateral.

Hrel
non-pert is much larger, dim

(
Hrel

non-pert

)
= O(e2S0). A similar result can be obtained for a

two-sided black hole, where the Hilbert space is also enlarged in the presence of an observer.
We explicitly compute the dimension of the Hilbert space in the presence of an observer in
the closed universe and two-sided black hole in section 4.

Geodesic bases, clock states, and the Wheeler-DeWitt constraint. The bulk state
that includes the observer can also be defined away from the asymptotic boundary of the
closed universe. By using our proposal for the gravitational path integral, we can ask questions
about what happens to the observer on time slices that probe the physics of the bulk. This
is necessary if we want to understand what happens to the observer in a Lorentzian closed
universe. The Lorentzian closed universe is an analytic continuation of the Euclidean spacetime
starting from the minimal closed geodesic that wraps the Euclidean cylinder [8, 45, 46, 76, 105];
in Lorentzian signature this time slice becomes a maximal closed geodesic wrapping around
the closed universe, see figure 2. Specifically, it is the time-reflection symmetric slice of a
closed Big Bang-Big Crunch universe which has no asymptotic future or past boundaries,
see figure 2. Consequently, in order to understand what happens to the observer in the
Lorentzian spacetime, we need to study the overlaps between the states

∣∣∣β,∆(i)
O

〉
defined on

asymptotic time-slices and the states defined on time-slices at finite Lorentzian time.
To start, we can compute the inner-product between a state defined on an asymptotic

boundary with a proper length β where the observer is inserted and the state defined along
the closed minimal geodesic on the Euclidean cylinder (i.e., the closed maximal geodesic
in the closed universe) whose length is b (see figure 4). To define this inner-product we
also have to specify how the worldline of the observer intersects this closed geodesic. One
can parametrize this intersection in terms of the angle that the worldline of the observer
makes (in the geodesic approximation) with the minimal closed geodesic. To simplify the
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computation, instead of using this angle, we will use the length u of the geodesic segment
that is perpendicular to the worldline of the observer at both ends of the segment and wraps
the cylinder once; this is the minimal geodesic segment which wraps the cylinder once while
starting and ending at some point on the worldline. The relation between this angle and
the length u is given by the hyperbolic law of cosines,

cos(θ) =

√
cosh(b)− cosh(u)

2 csch
(
b

2

)
. (3.9)

We will denote the resulting state on the closed minimal geodesic by |b,∆(i)
O , u⟩.

As shown in figure 4, we can decompose the hyperbolic geometry associated with the
overlap ⟨b,∆(i)

O , u|β,∆(j)
O ⟩ in terms of a Hartle-Hawking wavefunction ϕβ(ℓi), with ℓi being

the renormalized length of the geodesic that starts and ends at the intersection between the
asymptotic boundary and the observer’s worldline, and a quadrilateral that has two right
angles on one of the edges with length u that is opposite to the geodesic with renormalized
length ℓi. Within this quadrilateral, all lengths and angles can be determined in terms of
ℓi, u, and b. Note that this quadrilateral has the same area as the quadrilateral bounded
by b, ℓi and half of the observer’s worldline, ℓ/2. This is because the area is completely
determined by the angles at the intersection between ℓ and the boundary particle. Let us
call Qb the quadrilateral which includes b, and Qu the quadrilateral which includes u. In
order to compute the overlap, we need the contribution of Qb to the path integral, which is
just the area AQb

= AQu . Computing AQu , we find that the overlap between the asymptotic
state and the state defined on the closed geodesic is〈

b,∆(i)
O ,u

∣∣∣β,∆(j)
O

〉
(3.10)

= δij

16

∫ ∞

−∞
dℓiφβ(ℓi)e

∆O log
(

e−
ℓi
2 sinh u

2

)
e−4e−

ℓi
2 cosh(b/2)

coth
1
2
(

u
2
)
sinh

1
2
(

b
2

)
2

1
4 (cosh(b)−cosh(u))

1
4
+O(e−2S0) ,

at leading order. The first exponential accounts for the weight of the worldline whose
renormalized geodesic length is determined by ℓi and u and, from a repeated application of
the hyperbolic law of cosines, is given by − log

(
e−ℓi sinh u

2

)
. The second exponential comes

from the two angle terms between the worldline of the observer and the geodesic of length ℓi,
which determine the area of the quadrilateral. The remaining u-dependent and b-dependent
measure factors account for the fact that the overlap

〈
β′,∆(i)

O

∣∣∣β,∆(j)
O

〉
in (3.6) is consistent

with (3.11) if a resolution of the identity is inserted in the
∣∣∣b,∆(i)

O , u
〉

basis.18

18This measure factor can also be derived by starting with the Weil-Petersson measure in terms of b and the
twist τ between the bra and ket boundaries, ΩW P = db∧ dτ . If we say that the relative twist is zero when the
observer’s worldline crosses b orthogonally, then more generally, the twist directly determines the angle at
which the observer’s geodesic meets b. Using (3.9), we can then solve for the twist, τ = τ(u, b), as a function
of b and u. Using hyperbolic trig-identities, we find the expression

τ(b, u) = log
(√

(cosh b− coshu) /2 + sinh(b/2)
)
− log (sinh(u/2)) .

Plugging this into the Weil-Petersson measure and then absorbing a square root of this measure into the

wavefunction
〈
b,∆(i)

O , u

∣∣∣β,∆(j)
O

〉
, we get the same factor as in (3.11).
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Here, we have normalized the states
∣∣∣b,∆(i)

O , u
〉

as

〈
b,∆(i)

O , u
∣∣∣b′,∆(j)

O , u′
〉
= δijδ(b− b′)δ(u− u′) +O(e−2S0) (3.11)

At a perturbative level, this implies that the state
∣∣∣β,∆(i)

O

〉
defined on the asymptotic

boundary can be expressed as a linear combination of states defined on the minimal closed
geodesic time slice:

∣∣∣β,∆(i)
O

〉
=pert.

1
16

∫ ∞

−∞
dℓiφβ(ℓi)

∫ ∞

0
du coth

1
2

(
u

2

)
e
∆O log

(
e−

ℓi
2 sinh u

2

)

×
∫ ∞

u
db

sinh
1
2
(

b
2

)
2

1
4 (cosh(b)− cosh(u))

1
4
× e−4e−

ℓi
2 cosh(b/2)

∣∣∣b,∆(i)
O , u

〉
. (3.12)

We can also do the reverse and express
∣∣∣b,∆(i)

O , u
〉

as a linear combination of asymptotic
states. This can be done more easily by looking at asymptotic states with a fixed ADM
energy,

∣∣∣E,∆(i)
O

〉
, which are related to the states with fixed proper length by

∣∣∣β,∆(i)
O

〉
=∫

dEρ0(E)e−βE
∣∣∣E,∆(i)

O

〉
.19 Thus,

∣∣∣b,∆(i)
O , u

〉
can be expressed as,

∣∣∣b,∆(i)
O ,u

〉
=pert.

coth
1
2
(

u
2
)
sinh

1
2
(

b
2

)
16×2

1
4 (cosh(b)−cosh(u))

1
4

∫
dE

ρ0(E)
γ∆(i)

O

(E,E)

∫
dℓiφE(ℓi)e

∆O log
(

e−
ℓi
2 sinh u

2

)

×e−e−4 ℓi
2 cosh(b/2)

∣∣∣E,∆(i)
O

〉
. (3.13)

Both equations (3.12) and (3.13) should be understood as a consequence of the Wheeler-
DeWitt constraint, which in a closed universe relates states on all spatial slices related
purely by bulk evolution (which are therefore equivalent under diffeomorphisms). They
are the closed universe analog of equation (2.11) which, in the context of two-sided black
holes, related the states defined on asymptotic boundaries to those defined on geodesic slices,
probing the black hole interior.

We now derive the non-perturbative corrections to equation (3.11). This can easily be
done by noticing that, for a given worldline of the observer, we can always choose the unique
geodesic ℓi that starts and ends at the location of the observer on the asymptotic boundary
in the preparation of the bra and is in the same homotopy class as the closed geodesic of
length b in the preparation of the ket (see figure 5). Thus, the surface bounded by the
geodesic of length ℓi and the closed geodesic of length b has the topology of a cylinder. For
this cylinder, we can use the same decomposition into a quadrilateral as the one used to
compute (3.11) and a Hartle-Hawking wavefunction that takes into account the contribution
of other topologies. All we need to do is replace φβ(ℓi) in (3.11) with

φβ(ℓi) =
∫
dEρ0(E)φE(ℓi)e−βE , (3.14)

19As we explained in section 2, in this convention, the states with fixed ADM energy are normalized as〈
E′,∆(j)

O

∣∣∣E,∆(i)
O

〉
= δ(E−E′)

ρ0(E) γ∆(E,E).

– 27 –



J
H
E
P
0
5
(
2
0
2
5
)
0
5
9

Figure 5. Non-perturbative corrections to the overlap ⟨b,∆(i)
O , u|β,∆(j)

O ⟩. The geodesic slice of length
b is depicted in green. Any higher-genus geometry contributing to the overlap can be decomposed
into a genus-zero quadrilateral similar to figure 4 and a region with a higher genus homologous to the
boundary. The contribution of geometries with higher topology is then encoded in the Hartle-Hawking
wavefunction.

where ρ0(E) is given by the average density of states (multiplied by e−S0) with higher topology
corrections included. A similar logic applies both when computing the coarse-grained value
of the overlap and when computing higher moments of such overlaps.20 Because non-trivial
contribution to all these statistics only involves the spectral correlators ρ0(E1) . . . ρ0(Ek), the
statistics agree with coarse-graining or ensemble-averaging the spectrum of a single theory. If,
for a moment, one assumes that the statistics of these inner products come from an ensemble
of theories that have a discrete spectrum {E0, E1, . . . } (or by coarse-graining this spectrum
in a single theory), then we can write the states defined on the closed geodesic in terms
of the states

∣∣∣Ei,∆(i)
O

〉
that capture the possible discrete values of the ADM energy on the

asymptotic boundary. For example, the non-perturbative version of equation (3.13) becomes

∣∣∣b,∆(k)
O ,u

〉
=non-pert

coth
1
2
(

u
2
)
sinh

1
2
(

b
2

)
16×2

1
4 (cosh(b)−cosh(u))

1
4

×
∑
Ei

1
γ∆(Ei,Ei)

∫
dℓiφEi(ℓi)e−ℓie

∆O log
(

e−
ℓi
2 sinh u

2

)
e−e−4 ℓi

2 cosh(b/2)
∣∣∣Ei,∆(k)

O

〉
.

(3.16)

This can be viewed as the non-perturbative generalization of the Wheeler-DeWitt constraint
in the presence of an observer we discussed above. A consequence of equation (3.16) is that

20For example, higher powers of the overlap
〈
b,∆(i)

O , u

∣∣∣β,∆(j)
O

〉
are thus determined by

〈
b,∆(i)

O , u

∣∣∣β,∆(j)
O

〉k

= δij

16

∫ ( k∏
i=1

dℓi

)
φβ(ℓ1) . . . φβ(ℓk)

×
k∏

i=1

e∆ log
(

e
−

ℓi
2 sinh u

2

)
coth 1

2
(

u
2

)
sinh 1

2
(

b
2

)
2 1

4 (cosh(b)− cosh(u)) 1
4
e−4e−ℓi/2 cosh(b/2)

 (3.15)

where φβ(ℓ1) . . . φβ(ℓk) is determined by the spectral correlator ρ0(E1) . . . ρ0(Ek) that includes higher topology
corrections.
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the states
∣∣∣b,∆(k)

O , u
〉

no longer form an orthogonal basis. Instead, just like the geodesic
states in two-sided black holes, these states form an overcomplete set of states that still allow
us to do concrete calculations to determine the state on a bulk slice in the presence of the
observer. While the assumption of a discrete energy spectrum seems strong at first sight, in
section 4 we will use the non-trivial statistics obtained from the gravitational path integral
to determine the dimension of the Hilbert space Hrel

non-pert and show that it is in fact finite.
Later, in section 5, we will show that these statistics are consistent with a semi-positive
definite inner-product in which one has to eliminate the null states — i.e., states with a
non-zero norm at the perturbative level that have zero norm once the inner-product is
modified at the non-perturbative level — to get a well-defined Hilbert space. There, we will
also comment on how to construct such null states — for instance, by taking non-trivial
combinations of the states

∣∣∣b,∆(k)
O , u

〉
.

Why stop at defining the states of the gravitational theory on a closed geodesic slice?
For example, we might be interested in characterizing the spatial slice on which the observer
resides at a Lorentzian time t shown by their clock. Suppose we define the state of the
observer’s clock at time t = 0 to be |Ot=0⟩ =

∑
i ci |∆i⟩ and the state at time t to consequently

be |Ot⟩ =
∑

i cie
−i∆it |∆i⟩. We will assume that in the state |β,Ot=0⟩ the observer is prepared

in such a way that their clock shows t = 0 on the minimal closed geodesic slice on the
Euclidean cylinder, which in Lorentzian signature corresponds to the maximal, time-reflection
symmetric slice of the crunching universe. We would like to once again characterize the
state at time t in terms of the proper length a of the geodesic time slice on which they
reside at time t and the angle at which the worldline of the observer intersects this geodesic
slice. We will denote this geodesic timeslice by Σ. Though dressing to the observer’s clock
only makes sense in Lorentzian signature, for computational purposes we can perform the
calculation in Euclidean signature first, where the slice Σ is at a time τ along the observer’s
worldline, and then analytically continue our result to Lorentzian signature, by setting
τ = −it, as shown in figure 6.

Σ starts and ends at the location of the observer, wrapping the closed universe once.
At t = 0, Σ is a minimal closed geodesic. For t ̸= 0 this geodesic is not smooth; rather,
it has a kink at the location of the observer. As we shall explain, the properties of Σ are
fully determined in terms of the state on the minimal closed geodesic that lies within the
same homotopy class — as above, we will take the length of this minimal closed geodesic
to be b.21 We can characterize how the worldline meets Σ in terms of their intersection
angle. This is once again determined by the length u of the geodesic that is perpendicular
to the worldline of the observer at both ends and that, together with the worldline segment
in between the two ends, forms a closed curve that is also in the same homotopy class as
Σ. As mentioned above, the value of u also determines the angle at which the worldline of
the observer meets the closed geodesic of length b.

When going from Euclidean to Lorentzian signature there is an additional subtlety —
the angle θ at which the worldline of the observer intersects the minimal closed geodesic of
length b has to be complexified and needs to take the form π

2 + iR in order for the observer’s

21Note that for 2D surfaces with constant negative curvature, there always exists a closed smooth geodesic
(whose length we call b) homotopic to Σ.
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Figure 6. A state on a closed geodesic time slice Σ homotopic to a minimal closed geodesic, whose
length is b (depicted in green), is characterized by its length a and by the angle between Σ and the
observer’s worldline. In general this geodesic is not smooth for τ ̸= 0 (Euclidean — left side) or
t ̸= 0 (Lorentzian — right side). The angle can again be specified in terms of the length of a geodesic
segment wrapping around the universe once and intersecting the observer’s geodesic perpendicularly
at both ends. The state on Σ is uniquely determined by the state on the minimal closed geodesic of
length b. To make the worldline path real in Lorentzian signature, one has to complexify the path in
Euclidean signature; for this reason, on the right side, we show the observer worldline by a dotted
curve, signifying that that part of the trajectory is complexified.

worldline to correspond to a real trajectory in Lorentzian signature. From (3.9), we see
that this can simply be achieved by taking u > b; while such a geometry does not make
sense purely in Euclidean signature, it can be achieved in a complexified geometry. Thus,
to prepare a state on the minimal geodesic slice in which the observer travels along a real
trajectory in Lorentzian signature, we set u > b in (3.16).

Having addressed this subtlety, we can now discuss how the state prepared on minimal
geodesic slices is related to the state defined at finite time. If we keep u fixed we can now
easily express the length a of Σ in terms of the Lorentzian proper time t measured along
the worldline, with t = 0 at the minimal closed geodesic slice,

cosh(a) = cosh(b)− sin(t)2 (cosh(u)− 1) . (3.17)

When b = u, the observer hits the time-reflection symmetric slice perpendicularly (i.e., it is
at rest), and we see that the size of the geodesic time slice vanishes (a = 0) at t = π

2 ; this
is because the observer at rest hits the crunch singularity at this time. Setting u > b the
observer leaves the time-reflection symmetric slice at an angle and we see that the size of the
geodesic time slice first vanishes at an earlier time. This is because the proper time that the
observer experiences until they hit the singularity decreases once they are no longer at rest.
Past the time at which the observer hits the singularity, we see that a < 0, and we can no
longer make sense of the spacetime as corresponding to a real Lorentzian geometry.

Since both the intersection angles with Σ and the length a of Σ are fully determined
in terms of b and u, the geometry between Σ and the closed geodesic of length b is rigid.
Therefore, by using (3.17), we can now express the state of the bulk and the observer |a,Ot, u⟩,
at a fixed proper Lorentzian time t, by replacing b in (3.13) in terms of a, t and u. Note that
even though t and ∆(i)

O are conjugate to each other, we are considering a limit where the
spacing of the eigen-energies of the clock is sufficiently dense and close to ∆O such that we can
keep t fixed while replacing ∆(i)

O by ∆O. We, therefore, obtained a new (over)complete basis of
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states, labeled by the time read by the observer’s clock. It would be interesting to understand
whether the overcompleteness of such states plays an important role in understanding the
fate of the observer close to the crunch singularity.22

4 The Hilbert space of quantum gravity from an observer’s point-of-view

In this section, we compute the dimension of the relational Hilbert space Hrel
non-pert using

the statistics of our modified inner product. As anticipated in section 3, we find that the
dimension of Hrel

non-pert is much larger than the dimension of Hnon-pert obtained in section 2.
We start with the simple closed universe case in section 4.1 before moving on to the more
involved two-sided black hole case in section 4.2.

We saw in section 3 that considering a finite window for the scaling dimension ∆O, and
accordingly labeling states by a bulk geodesic length and the time read by the observer’s
clock is important when calculating correlation functions because operator insertions must
be appropriately dressed to the observer’s worldline. However, in the present section, we are
only interested in computing properties of the Hilbert space Hrel

non-pert and not observables.
For this purpose, we can simplify our analysis by working with the basis of asymptotic
states discussed at the beginning of section 3, which are entirely specified by their boundary
conditions at the asymptotic boundary. In particular, we will take the scaling dimension
∆O of the observer operator to be fixed for all states. We will go back to the study of
dressed observables in section 6. Moreover, we will focus on the generic case of JT gravity
coupled to matter and restrict our attention to an arbitrary but finite energy window, for
which the non-perturbative Hilbert space is finite-dimensional. We can then fix the length
of the asymptotic boundary to be β for all states and simply label states by the indices of
matter insertions at the asymptotic boundary.

In order to prove that Hrel
non-pert is, in fact, a Hilbert space, we need to show that the inner

product computed by the gravitational path integral using our new rules is positive-definite.
We will show in section 5 that the inner product is, in fact, positive semi-definite due to
the presence of null states and Hrel

non-pert is a well-defined Hilbert space after quotienting out
the set of null states. We can ignore these details for now because the resolvent calculation
of dim

(
Hrel

non-pert

)
is valid at the level of vector spaces and is thus independent of the

positive-definiteness of the inner product.

4.1 Closed universe

Let us start by examining a closed universe in JT gravity coupled to matter. The most
generic state is prepared by the path integral with one boundary of length β where we insert
an operator OO associated with the observer and a matter operator Oi carrying an index i,
see figure 7. We will take the dimensions of the two operators to be ∆O and ∆m, respectively.
We will label such a state by |ψi⟩, where i = 1, . . . ,K is a flavor index of the matter operator.
We will take the two insertions to be antipodal on each boundary, namely βl = βr = β/2,
where βl and βr are boundary lengths between the insertions of OO and Oi to the left and

22We will further comment on this topic in section 6.1 where we discuss how correlation functions measured
along the worldline of the observer can be used as a probe of this singularity.
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Figure 7. Path integral preparing a generic closed universe state |ψi⟩ in the presence of an observer
and a matter insertion labeled by i. Left: boundary conditions for the path integral, with a worldline
for the observer (depicted in red) and the insertion of a matter operator with flavor i and scaling
dimension ∆m at the asymptotic boundary. The insertions are at antipodal points. Right: the
gravitational path integral prepares a state for the closed universe satisfying these boundary conditions.
We indicate here the energies s1 and s2 of the patches to the left and right of the observer. We omit
these labels in the rest of the figures in this section, but the same convention is used in all geometries,
leading to equations (4.1) and (4.2).

right of the observer, respectively. As we will see, for sufficiently large K, this set of states
spans the entire quantum gravity non-perturbative Hilbert space in an arbitrary but finite
energy window. Considering states with arbitrary βl and βr would not enlarge the Hilbert
space, but simply give us a different basis.23

We will also assume ∆m,∆O ≫ S0. This assumption guarantees that we can safely neglect
contributions to the path integral with intersecting geodesics because they are exponentially
suppressed in ∆m, ∆O and, therefore, subdominant with respect to higher genus contributions
with no intersections. As we will see, this assumption greatly simplifies our computation of
the dimension of Hrel

non-pert. On the other hand, we expect the final answer for dim
(
Hrel

non-pert

)
to be independent of the size of the scaling dimensions ∆O,∆m, as we will discuss at the
end of the present subsection.

Let us now compute the dimension of the non-perturbative, relational Hilbert space
Hrel

non-pert for an observer in a closed universe using a resolvent calculation. Imposing that
observer worldlines must connect between a bra and the corresponding ket, the leading
contribution in the gravitational path integral to the connected n-th moment of an overlap,24

⟨ψi|ψk⟩⟨ψk|ψl⟩ . . . ⟨ψm|ψj⟩conn ≈ Zclosed
n δij is given by a genus-zero pinwheel geometry with

2n boundaries, see figure 8.
Notice that this geometry is analogous to that depicted in equation (2.38) and relevant

for the calculation of dim (Hnon-pert) in the two-sided black hole case (see appendix B). The
only differences are that the geometry computing the n-th momentum now has 2n boundaries
(instead of n boundaries), and that the type of geodesic connecting the asymptotic boundaries
now alternate between matter and observer geodesics. Just like in equation (2.38), this surface
has two connected patches separated from each other by matter and observer geodesics, and

23In terms of the infinite-dimensional, perturbative Hilbert space Hrel
pert, fixing βl = βr = β/2 restricts us to

a subspace of the full Hilbert space.
24The overline indicates that the quantity is computed using the gravitational path integral and therefore

averaged over the dual matrix ensemble. Note that indices are not summed over in this formula.
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Figure 8. Genus-zero pinwheel geometry contributing to the n = 3 moment of an overlap
⟨ψi|ψj⟩⟨ψj |ψk⟩⟨ψk|ψi⟩ (no sum over indices). The observer’s worldlines (depicted in red) must
connect between a bra and the corresponding ket. Matter geodesics (depicted in green) can connect
between arbitrary bras and kets.

therefore two different energies to be integrated over. The connected contribution Zclosed
n ,

which will play a central role in our resolvent calculation, thus takes the form25

Zclosed
n = e(2−2n)S0

∫
ds1ds2ρ0(s1)ρ0(s2)

[
e−

βs21
2 e−

βs22
2 γ∆O

(s1, s2)γ∆m(s1, s2)
]n

= e2S0

∫
ds1ds2ρ0(s1)ρ0(s2)x̃n(s1, s2)

(4.1)

where we took into account that the pinwheel in figure 8 has genus zero and 2n boundaries,
and in the second equality we defined

x̃ = e−2S0e−
βs21
2 e−

βs22
2 γ∆O

(s1, s2)γ∆m(s1, s2). (4.2)

The normalization factors γ∆O
, γ∆m associated respectively with the observer and matter

worldlines are given in equation (2.24). Notice that each x̃ is associated with a pair of
boundaries (namely, with an overlap), each boundary has length β, and we used E = s2/2
like in section 2.

Let us now consider a set of K states {|ψi⟩} with i = 1, . . . ,K, define

d2 ≡ e2S0

∫
ds1ds2ρ0(s1)ρ0(s2) (4.3)

similar to equation (2.44), and work in the regime K → ∞, e2S0 → ∞ with K/e2S0 = O(1).
Using the definition (2.40) of the resolvent and computing moments of the overlap using the

25All the integrals over energies (i.e., over s) in this section are restricted to an arbitrary but finite energy
window.
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gravitational path integral, the resolvent takes the diagrammatic form

i jR i j= i j

?

i

?

j

?
++ +  ...

i j= i j+ ji+ +

i j+ +  ...

= i j i j+ i j+ +  ...R R

R

(4.4)

In the last equality, we rearranged the expansion in terms of the number of boundaries to
which the first boundary is connected. This gives us a Schwinger-Dyson equation:

Rij(λ) =
δij

λ
+ 1
λ

∞∑
n=1

Zclosed
n Rn−1(λ)Rij(λ) (4.5)

where Zclosed
n is given in equation (4.1), we introduced the overline to indicate that the

resolvent is computed using the gravitational path integral (and therefore averaging over the
dual ensemble of random matrices), and we defined the trace of the resolvent R(λ) =

∑
iRii(λ).

Taking the trace on both sides, using equation (4.1), and performing the sum over n, we obtain

R(λ) = K

λ
+ e2S0

λ

∫
ds1ds2ρ0(s1)ρ0(s2)

R(λ)x̃(s1, s2)
1−R(λ)x̃(s1, s2)

. (4.6)

Given R(λ) in equation (4.6), we can compute the rank of the Gram matrix M of
overlaps, i.e., the dimension of the Hilbert space Hrel

non-pert(K) spanned by the K states
using equation (2.42). Notice that the analytic structure of the resolvent is identical to that
encountered in appendix B when computing dim (Hnon-pert) in the two-sided black hole case.
In particular, R(λ) has a branch cut on the positive real axis, it has no pole for K < d2, it
has a pole at λ = 0 for K > d2, and it behaves as R(λ) ∼ K/λ for λ → ∞ (see [74] and
appendix A for details). Therefore, for K < d2, the integral over the contour C = C0 ∪ C∞
depicted in figure 3 receives a contribution only from C∞ (the counterclockwise contour
at infinity), and we obtain

dim
(
Hrel

non-pert(K)
)
= K

2πi

∮
C

dλ

λ
= K, K < d2. (4.7)

On the other hand, for K > d2, R(λ) has a pole at λ = 0, and the integral receives
contributions from both C∞ and the clockwise contour C0 around the pole at the origin. The
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integral over C∞ is the same as equation (4.7) and gives a contribution equal to K. For the
integral over C0, the presence of the pole in R(λ) implies that the integrand in the second
term of equation (4.6) is independent of λ near λ = 0, and we obtain

1
2πi

∮
C0
dλR(λ) = K − d2

2πi

∮
C0

dλ

λ
= d2 −K, (4.8)

where d2 is defined in equation (4.3). We thus find dim
(
Hrel

non-pert(K)
)
= d2 for K > d2.

In summary, the dimension of the non-perturbative Hilbert space spanned by K matter
states and relevant to describe relational dynamics with respect to an observer in the closed
universe is given

dim
(
Hrel

non-pert(K)
)
=

K K < d2

d2 K > d2
(4.9)

A few comments are in order. First, the result (4.9) is similar to that obtained for
the Hilbert space of a black hole spanned by microstates of bulk matter [16, 17, 26, 27].
In particular, we found that different matter states that are orthogonal to each other at
the perturbative level are not orthogonal non-perturbatively due to spacetime wormhole
corrections to the inner product. If we consider K < d2 matter states, they span a non-
perturbative Hilbert space of dimension K, and there are no null states. But if we choose
K > d2, the non-trivial overlaps between matter states lead to the existence of null states
signaled by the pole of R(λ) at λ = 0. The residue K−d2 gives the number of null states among
the K basis states considered. The K matter states are overcomplete [16, 17, 26, 27] in the
non-perturbative gravitational Hilbert space Hrel

non-pert, which has dimension dim
(
Hrel

non-pert

)
=

d2.26 We will comment further about null states in this setup in section 5. Second, notice that,
unlike the global non-perturbative Hilbert space Hnon-pert of the closed universe in the absence
of an observer considered in section 2.3, the non-perturbative relational Hilbert space is
non-trivial. Remember that Hrel

non-pert should be regarded as the Hilbert space of gravitational
degrees of freedom that an observer in the bulk can interact with, and therefore, the one
relevant for the description of the experience of the bulk observer. Third, it is easy to show
that if instead of considering JT gravity coupled to matter, we considered pure JT gravity, we
would have obtained a quantum gravity relational Hilbert space of dimension d. This is due to
the additional constraint that the energies on the two sides of the observer must be equal (i.e.,
s1 = s2) because there is a single connected bulk patch wrapping around the closed universe.

Let us also comment on the assumption ∆m,∆O ≫ S0 that allowed us to neglect
contributions to the path integral in which worldlines intersect. Relaxing this assumption and
taking intersecting geodesics into account would certainly modify the resolvent and its trace
R(λ). However, our calculation of the dimension of Hrel

non-pert only relied on the asymptotic
behavior R(λ) ∼ K/λ as λ→ ∞ and on its analytic structure — namely that the only pole
is at λ = 0 when K > d2 and the only branch cut on the positive real axis [74]. Although

26Notice that the dimension of Hrel
non-pert is finite only when restricting to an arbitrary but finite energy

window. From equation (2.10) we see that the integral in equation (4.3) diverges if we consider an infinite
energy window.
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including corrections from intersecting geodesics modifies the resolvent, we expect the analytic
properties in the neighborhood of λ = 0, and therefore the result (4.9), to remain unchanged.27

Finally, we remark that one interesting feature of the full quantum gravity relational
Hilbert space Hrel

non-pert in the presence of matter is that it factorises into a Hilbert space to
the right of the observer and a Hilbert space to the left of the observer:

Hrel
non-pert = Hrel

non-pert,l ⊗Hrel
non-pert,r. (4.10)

This result, which we explicitly derive in appendix C.1, also holds in the presence of an arbitrary
number of matter insertions. This contrasts with pure JT gravity, where dim

(
Hrel

non-pert

)
= d

and the Wheeler-DeWitt constraint guarantees the existence of a single, non-factorised Hilbert
space to the right and left of the observer. The latter case is analogous to the non-factorised,
d-dimensional Hilbert space for a two-sided black hole in the absence of an observer or matter,
and it is due to the additional constraint that the energies to the left and right of the observer
are equal. As we will argue in section 7.2, the result (4.10) suggests that, in the JT gravity
with matter setup, a putative holographic dual description living on the worldline of the
observer would consist of two entangled, non-interacting copies of a holographic theory.

4.2 Two-sided black holes

Let us now examine the case of a two-sided black hole in JT gravity coupled to matter. In the
presence of the worldline of an observer, the most generic state one can consider is prepared
by the insertion of a matter operator Oi carrying an index on each side of the observer, see
figure 9. We will label such a generic state by |ψii′⟩, where i and i′ are the indices of the
matter insertions on the right and left side of the observer, respectively.28 Similar to the
closed universe case, throughout this section, we will take each boundary segment in the
preparation of the state to have the same length β/8, where β is the length of a full boundary,
see figure 9.29 We will further assume that the dimension of the matter operators is the same
for all insertions — i.e., ∆i ≡ ∆m for all i — and that, just like in the closed universe case,
the dimension of all the operators considered is large, ∆m,∆O ≫ S0 and we can therefore
neglect contributions to the path integral where geodesics intersect. As we have discussed in
section 4.1, we do not expect this assumption to affect the analytic structure of the resolvent
and, therefore, the computation of the dimension of Hrel

non-pert.
Let us now compute the dimension of the Hilbert space seen by an observer using a

resolvent calculation. Imposing that observer worldlines connect a bra to the corresponding
ket and that no geodesics intersect, the leading contribution to the connected n-th moment

27The universality of the residue of the resolvent at λ = 0 is also manifest if we make the scaling dimensions
of all operator insertions different from each other or if we change other details in the preparation of the states
|ψi⟩ whose statistics are captured by R(λ) [74].

28Notice that the ordering of the insertions is important, because it determines the specific gluing of the
asymptotic boundary and observer worldline when computing overlaps. For example, in the ∆m,∆O ≫ 1
limit of our interest, ⟨ψ12|ψ21⟩ ≈ 0 perturbatively, because the geodesics connecting the matter insertions to
each other on the disk need to cross the observer worldline, and are therefore exponentially suppressed in ∆m

and ∆O.
29Like in the closed universe case, this specific set of states spans only a subspace of the perturbative

relational Hilbert space Hrel
pert, but is an overcomplete basis for the non-perturbative relational Hilbert space

Hrel
non-pert.
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Figure 9. Path integral preparing a state |ψii′⟩ for the two-sided black hole in the presence of an
observer and matter insertions to the right and left of the observer labeled by i and i′. Every boundary
segment in the preparation of a state is taken to have length β/8. Left: boundary conditions for the
path integral, with a worldline for the observer (depicted in red) and the insertion of matter operators
with flavors i and i′ and scaling dimension ∆m at the asymptotic boundary. Right: the gravitational
path integral prepares a state for the two-sided black hole satisfying these boundary conditions. We
indicate here the energies s1, s2, s3, s4 of the four patches. We omit these labels in the rest of the
figures in this section, but the same convention is used in all geometries, leading to equations (4.11)
and (4.12).

Figure 10. Genus n− 1 geometries with n boundaries contributing to the n-th moment of an overlap
in the two-sided black hole in the presence of an observer. The observer’s worldlines (depicted in
red) must connect between a bra and the corresponding ket. Matter geodesics (depicted in green)
can connect between arbitrary bras and kets. Geodesics do not intersect in these leading, connected
contributions. (a) Genus g = 1, 2-boundary geometry contributing to the square of an overlap
|⟨ψjj′ |ψii′⟩|2. (b) Genus g = 2, 3-boundary geometry contributing to the n = 3 moment of an overlap
⟨ψjj′ |ψii′⟩⟨ψii′ |ψkk′⟩⟨ψkk′ |ψjj′⟩ (no sum over indices).

of an overlap is given by a surface with n boundaries and genus n− 1, see figure 10. This
geometry can be built by considering two copies of a n-boundary pinwheel geometry where
each boundary is composed by a segment associated with an asymptotic boundary and a
segment associated with the worldline of an observer, see figure 11. The genus n− 1 surface
is then obtained by gluing the two pinwheels along the observer worldlines. It is then clear
that such a geometry has four different connected patches (two for each pinwheel) separated
from each other by the observer and matter geodesics, and therefore four different energies to
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Figure 11. The genus n− 1, n-boundary geometry contributing to the n-th moment of an overlap
can be obtained by gluing together two genus-0 pinwheel geometries with n boundaries. Here we
depict the pinwheels and the resulting glued geometry for n = 3. Each boundary of the pinwheels
is composed of a segment of asymptotic boundary and a segment of observer’s worldline. The two
pinwheels are glued together along the observer’s worldlines as depicted.

be integrated over. The leading contribution to the connected n-th moment of an overlap30

ZBH
n ≈ ⟨ψii′ |ψjj′⟩ . . . ⟨ψmm′ |ψii′⟩ is then given by

ZBH
n ≡ e[2−2(n−1)−n]S0

∫
ds1ds2ds3ds4ρ0(s1)ρ0(s2)ρ0(s3)ρ0(s4)

×
[
e−

β(s21+s22+s23+s24)
8 γ∆m(s1, s2)γ∆m(s3, s4)γ∆O

(s2, s4)
]n

= e4S0

∫
ds1ds2ds3ds4ρ0(s1)ρ0(s2)ρ0(s3)ρ0(s4)ỹn(s1, s2, s3, s4)

(4.11)

where we used χ = (2− 2g−n) for the Euler characteristic (our geometry has genus g = n− 1
and n boundaries) and in the second equality we defined

ỹ(s1, s2, s3, s4) = e−3S0e−
β(s21+s22+s23+s24)

8 γ∆m(s1, s2)γ∆m(s3, s4)γ∆O
(s2, s4). (4.12)

γ∆m , γ∆O
are the normalization factors defined in equation (2.24).

Let us consider a set of K2 states {|ψii′⟩} where i, i′ = 1, . . . ,K, and denote the overlap
between two states by Mii′,jj′ = ⟨ψii′ |ψjj′⟩. We will work in the regime K → ∞, e2S0 → ∞
with K/e2S0 = O(1). Similar to equations (2.44) and (4.3), let us define

d4 ≡ e4S0

∫
ds1ds2ds3ds4ρ0(s1)ρ0(s2)ρ0(s3)ρ0(s4). (4.13)

We assume once again that the integrals over energies are to be restricted to an arbitrary
but finite energy window. The resolvent is now defined as31

Rii′,jj′(λ) =
( 1
λ1−M

)
ii′,jj′

= δijδi′j′

λ
+ 1
λ

∞∑
n=1

(Mn)ii′,jj′

λn
. (4.14)

30Notice that indices are not being summed over in this formula.
31The identity in this space is given by 1ii′,jj′ = δijδi′j′ .
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Using the gravitational path integral to compute moments of the overlap as explained above,
we can rewrite equation (4.14) in terms of spacetime geometries:32

(4.15)

In the last equality, we rearranged the expansion in terms of the number of boundaries to which
the first boundary is connected. The corresponding Schwinger-Dyson equation takes the form:

Rii′,jj′(λ) =
δijδi′j′

λ
+ 1
λ

∞∑
n=1

ZBH
n Rn−1(λ)Rii′,jj′(λ) (4.16)

where ZBH
n is given by equation (4.11), we introduced again the overline to indicate that the

resolvent is computed using the gravitational path integral, and R(λ) =
∑K

i,i′=1Rii′,ii′(λ) is the
trace of the resolvent. Taking the trace of equation (4.16) and performing the sum, we obtain

R(λ) = K2

λ
+ e4S0

λ

∫
ds1ds2ds3ds4ρ0(s1)ρ0(s2)ρ0(s3)ρ0(s4)

R(λ)ỹ(s1, s2, s3, s4)
1−R(λ)ỹ(s1, s2, s3, s4)

. (4.17)

With this result in hand, we can now calculate the dimension of the Hilbert space Hrel
non-pert(K)

spanned by the K states, which is related to the trace of the resolvent by equation (2.42).
Notice that the structure of the Schwinger-Dyson equation (4.17) is analogous to that

obtained in the closed universe case in section 4.1, and in the computation of dim (Hnon-pert)
in appendix B. Therefore, the analytic properties of R(λ) are also similar (see [74] and
appendix A for details). The calculation of dim

(
Hrel

non-pert(K)
)

is then completely analogous
to the closed universe case, and we will skip the details here. In the end, we find that the
dimension of the Hilbert space spanned by the K matter states and relevant to describe
relational dynamics with respect to a bulk observer in the two-sided black hole case is

dim
(
Hrel

non-pert(K)
)
=

K2 K2 < d4

d4 K2 > d4
(4.18)

32The notation used in the diagrammatic expansion for the 4-index resolvent is completely analogous to
that explained in Footnote 13 for the 2-index resolvent.
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which shows that the underlying non-perturbative, relational quantum gravity Hilbert space
has dimension dim

(
Hrel

non-pert

)
= d4. Notice that this is again much larger than the Hilbert

space of the two-sided black hole Hnon-pert in the absence of an observer computed in
appendix B, which had dimension dim (Hnon-pert) = d2.

Computing the dimension of the Hilbert space in pure JT gravity (in the absence of matter)
in the presence of an observer gives dim

(
Hrel

non-pert

)
= d2 as opposed to dim (Hnon-pert) = d

in the absence of an observer. This is due to the additional constraint s1 = s2 and s3 = s4,
namely that there is only one connected patch of spacetime to the left of the observer, and
one to the right of the observer. Just like in the closed universe case, we expect that relaxing
the technical assumption that ∆m,∆O ≫ S0 does not affect the analytic structure of the
resolvent, and therefore the result (4.18).

Finally, the non-perturbative quantum gravity relational Hilbert space also factorises. In
the presence of matter, we have (this result is derived in appendix C.2)

Hrel
non-pert = Hrel

non-pert,R ⊗Hrel
non-pert,r ⊗Hrel

non-pert,L ⊗Hrel
non-pert,l, (4.19)

where Hrel
non-pert,R, Hrel

non-pert,L are associated with the right and left asymptotic boundaries,
and Hrel

non-pert,r, Hrel
non-pert,l with the right and left sides of the observer, respectively. For pure

JT gravity without matter, the d2-dimensional Hilbert space Hrel
non-pert factorises into two

Hilbert spaces: one associated with the region between the observer and the left asymptotic
boundary, and the other with the region between the observer and the right asymptotic
boundary. This is because of the additional constraints that s1 = s2 and s3 = s4 arise in the
absence of matter. As we will discuss in section 7.2, the result (4.19) for factorisation also
suggests that a putative dual holographic description of the two-sided black hole with matter
in the presence of an observer consists of four non-interacting holographic theories: two living
on the two asymptotic boundaries, and two on the worldline of the observer.

5 Positivity of the inner product and null states

In the previous section, we computed properties of different Hilbert spaces in the presence of
an observer. Technically speaking, however, we still did not show that the vector spaces Hrel

pert
and Hrel

non-pert are Hilbert spaces, because we did not prove that the modified inner product
in the presence of an observer introduced in section 3 is positive semi-definite. We turn now
to filling this logical gap, and, as a by-product, we will find a simple description of the null
states in the various non-perturbative Hilbert spaces in the presence of an observer.

5.1 Inner product is positive semi-definite

We will discuss the inner product in the closed universe case, leaving the two-sided black
hole case, discussed in section 4.2, as an exercise for the reader since the discussion is quite
similar. We saw in section 3 that we can describe the set of states with an observer by
their asymptotic boundary conditions, with possible matter insertions along the asymptotic
boundary. We could also describe the states in terms of the geometry and the observer
state on a closed geodesic slice. In this section, we will find it more convenient to work
with asymptotic states, although everything we say can be extended to closed geodesic slices
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by using the transform in (3.12) (or its generalization when matter is also present). Such
asymptotic states are labeled by the two asymptotic lengths, βl and βr, which lie between the
observer and the matter insertion. The matter insertions will also be labeled by the flavor
index, which runs over i = 1, . . . ,K. We denote these states by |βl, βr, i⟩. Note that this
set of states spans the whole perturbative Hilbert space. This is unlike our choice of states
in section 4, where we restricted to the subspace of the perturbative Hilbert space where
βl = βr for convenience since, as far as the non-perturbative Hilbert space is concerned, both
sets of states are vastly over-complete and span the full space.

The non-perturbative inner-product in the presence of an observer is defined by a path
integral in the presence of boundary conditions given by

〈
βl, βr,∆i

∣∣β′l, β′r,∆j
〉

H =
∫
dℓ e−∆Oℓ ℓℓ

βl βri

jβ′l β′r

. (5.1)

As in [38], and as we mentioned in section 2 and the discussion around (3.14), we will find it
useful to use the matrix integral perspective on these overlaps. In equations (3.15) and (3.16),
the corrections due to higher topology of the overlaps between the closed geodesic state∣∣∣b,∆(i)

O , u
〉

and the asymptotic state
∣∣∣β,∆(j)

O

〉
were interpreted as coming from a random

average over possible boundary Hamiltonians, H. Similarly, here, we interpret the non-
perturbative corrections to the overlaps in (5.1) as also coming from a random average over
possible boundary theories (i.e., a matrix integral). The subscript H on the left-hand side
of (5.1) is then to denote that these boundary conditions define an operator in the matrix
integral, which depends upon a draw of the Hamiltonian H from the ensemble. To leading
order in the genus expansion, this inner product reads

〈
βl, βr,∆i

∣∣β′l, β′r,∆j
〉

H =
∫
dℓ e−∆Oℓ ℓℓ

βl βri

jβ′l β′r

=
∫
dsldsr ρ0(sl)ρ0(sr) e−(βl+β′

l)
s2

l
2 −(βr+β′

r)
s2r
2 × γ∆O

(sl, sr)×
(
δijγ∆i

(sl, sr)
)
. (5.2)

As in previous sections, the overline denotes that we are computing quantities using the
gravitational path integral or, equivalently, we are averaging the quantities over the dual
ensemble. We can re-arrange this equation for the inner product into bras and kets to make
the inner product structure more manifest. Namely we can define wave-functions

⟨sl, sr,∆i|βl, βr,∆i⟩ ≡ e−βl
s2

l
2 −βr

s2r
2 δij

√
γ∆i

(sl, sr). (5.3)
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Then equation (5.2) may be written suggestively as〈
βl, βr,∆i

∣∣β′l, β′r,∆j
〉

H

=
∑
i′j′

∫
dsldsr ds

′
lds

′
r ⟨βl, βr,∆i|sl, sr,∆i′⟩ gi′j′

∆O
(sl, sr; s′l, s′r)

〈
s′l, s

′
r,∆j′

∣∣β′l, β′r,∆j
〉
, (5.4)

where

gij
∆O

(sl, sr; s′l, s′r) ≡ δijδ(sl − s′l)δ(sr − s′r)ρ0(sl)ρ0(sr)γ∆O
(sl, sr). (5.5)

We, therefore, see that the perturbative inner product expressed in the |sl, sr,∆i⟩ basis is
diagonal and furthermore has positive eigenvalues. Therefore, we confirmed that Hrel

pert is a
well-defined Hilbert space. This result was expected because the perturbative inner product
on the subspace of perturbative states with an observer is unmodified by our new rules
for the gravitational path integral.

To include higher genus effects and study the non-perturbative inner product, we now
rely on the mapping between this model and a dual matrix integral, which captures all
non-perturbative effects. Indeed, since we are ignoring all worldline crossings, all possible
relevant contractions on higher-genus surfaces (including in calculations of higher moments
of the inner product matrix) are captured by the JT matrix model of [13] together with K

operators Oi for i = 1, . . . ,K which model the matter. As pointed out in section 4 of [102],
these matter operators have matrix elements that are drawn from a Gaussian ensemble
of mean zero and variance

⟨Ea1 | Oi |Ea2⟩ ⟨Ea3 | Oj |Ea4⟩ ≡ Oi
a1a2O

j
a3a4 = δijδa1a4δa2a3γ∆i

(Ea1 , Ea2). (5.6)

As discussed in [38] and at the end of section 2.1, when the matter fields on a geodesic slice are
in their ∆ = m = 0 ground state, fixed ℓ boundary conditions correspond non-perturbatively
to an insertion of φ̃√

2H(ℓ).33 The following diagram can then be computed to all orders in
the genus expansion by inserting into the matrix integral the operator

ℓℓ

βl βri

jβ′l β′r

= Tr
(
φ̃√

2H(ℓ)e−β′
lHOje−β′

rH φ̃√
2H(ℓ)e−βrHOie−βlH

)
, (5.7)

where we take a trace since the boundary conditions form a closed cycle. To write this
expression in a form more akin to (5.4), it is convenient to introduce a doubled Hilbert space
so that operators, such as Oi, get mapped to entangled states as

Oi =
∑
a,b

Oi
ab |Ea⟩ ⟨Eb| →

∑
a,b

Oi
a,b |Ea⟩l |Eb⟩r ≡

∣∣∣Oi
〉

lr
. (5.8)

33Here φ̃√
2E(ℓ) is the length wavefunction given in (2.9) and φ̃√

2H(ℓ) is the corresponding function of the
Hamiltonian.
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One can then write expression (5.7) more suggestively as

ℓℓ

βl βri

jβ′l β′r

=
〈
βl, βr,Oi

∣∣∣ψHl
(ℓ)⊗ ψHr(ℓ)

∣∣∣β′l, β′r,Oj
〉

lr
, (5.9)

where
∣∣βl, βr,Oi

〉
≡ e−βlHl−βrHr

∣∣Oi
〉
. Integrating against e−∆Oℓ, we find〈

βl, βr,∆i

∣∣β′l, β′r,∆j
〉

H =
〈
βl, βr,Oi

∣∣∣ g∆O
(Hl, Hr)

∣∣∣β′l, β′r,Oj
〉

lr
(5.10)

where34

g∆O
(Hl, Hr) = γ∆O

(Hl, Hr). (5.11)

Since g is a positive definite matrix on the tensor-product Hilbert space Hrel
non-pert =

Hrel
non-pert,l ⊗ Hrel

non-pert,r, then the non-perturbative modified inner product in the presence
of an observer is also positive semi-definite. The reason this inner product is only positive
semi-definite and not positive definite is because of the presence of null states, which we
describe in the next subsection.

First, however, we briefly point out what the operator g∆O
would be if we had treated

the observer like yet another matter operator, with matrix elements pulled from the Gaussian
ensemble. In that case, the boundary conditions would just be two disconnected circles, each
with two green dots — one for the observer insertion and one for the matter insertion. We
can still introduce the left and right Hilbert spaces, and after doing so, it is not hard to
see that, as a consequence of the Gaussian statistics of the operator, g∆O

(Hl, Hr) as defined
in (5.11) should be replaced by the projector

g∆O
(Hl, Hr) → |OO⟩⟨OO|lr . (5.12)

This inner product tells us that all perturbative states in Hlr which are orthogonal to |OO⟩lr

become null, and so the non-perturbative Hilbert space is one-dimensional. Equation (5.12)
clearly explains how replacing the observer with a “regular” matter particle reduces the
non-perturbative Hilbert space to one dimension. The replacement in (5.12) also makes
clear what one needs to do in order to return to the inner product in (5.11): average over
the matrix elements of the observer’s wavefunction coefficients, OO(El, Er), used to define
|OO⟩ =

∑
El,Er

OO(El, Er) |El⟩ |Er⟩. Namely, using the formula (5.6), we see that

|OO⟩⟨OO|lr = γ∆O
(Hl, Hr). (5.13)

The inner product in the presence of an observer is, in this sense, an average over non-
perturbative Hilbert spaces without an observer. This result also clarifies how to compute

34We remind the reader that we are viewing γ∆O
(Hl, Hr) as a matrix function of the two operators Hl ≡ H⊗1

and Hr ≡ 1⊗H which act on the doubled Hilbert space.
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quantities relevant to describing the experience of an observer from a matrix integral point
of view. First, we identify a given Gaussian matrix OO describing matter to represent
our observer. Second, we compute the observable of interest in a single realization of the
Hamiltonian and matter ensembles. Finally, we average over the OO ensemble. Notice
that we average only over OO and not the Hamiltonian or other matter matrix ensembles.
This corresponds to the special treatment reserved to the observer in our rules for the
gravitational path integral.

5.2 Null states

Armed with formula (5.10), for the non-perturbative inner product in the presence of an
observer, we can now simply read off the null states. By “null states”, we have in mind states
in the perturbative Hilbert space that have zero norm with respect to the non-perturbative
inner product. States in the perturbative Hilbert space in the presence of an observer form a
continuum, labeled by the continuous labels βl and βr (or El and Er), along with the discrete
index labeling the flavor of matter particle. For analyzing null states, since the inner product
operator g∆O

(Hl, Hr) is a function of just Hl and Hr, it is convenient to work with the basis
of states labeled by continuous energies El and Er. We can then write a general state, |ψ⟩,
in the perturbative Hilbert space as a linear superposition of such states as

|ψ⟩ =
∑

k

∫
dEldEr ψ̂∆k

(El, Er) |El, Er,∆k⟩ . (5.14)

For a given draw of the ensemble of JT Hamiltonians H together with the Gaussian-distributed
matrix elements for the matter, the spectrum of Hl and Hr will be discrete. Thus, when we
compute the norm of the general state in (5.14) using the inner product in (5.10), we find

⟨ψ|ψ⟩ =
∑

k,k′,a,b

(
ψ̂∆k

(Ea, Eb)
)∗
ψ̂∆k′

(Ea, Eb)×
(
O∆k

ab

)∗
O∆k′

ab × g∆O
(Ea, Eb). (5.15)

Clearly, null states can be formed just by demanding that ψ̂∆k
have no support on the

discrete energy spectrum of either Hl or Hr. Furthermore, if we allow the matter flavor
to vary, we see that there is an even larger multiplicity of null states due to the fact that
g∆O

(Hl, Hr) does not have a label for the matter index.
This pattern of null states should be directly compared to what was found for a two-sided

black hole in the presence of matter but without an observer in [38]. There, again, the
perturbative Hilbert space is labeled by three numbers |El, Er,∆i⟩, where El and Er are
continuous labels at the disk level, as reviewed in section 2.1. Non-perturbatively, however,
the Hilbert space becomes labeled by a (random) set of discrete numbers,

∣∣Ei
l , E

j
r

〉
, and states

are not labeled by the flavor/matter index. This means the null states in the two-sided
black hole with matter but without an observer are of the same structural form as the
closed universe with matter and an observer. Of course, this is not a coincidence. By the
formula in equation (5.1), we see that we can think of the closed universe with an observer
as a two-sided black hole where the two asymptotic boundaries are replaced by geodesic
worldlines and then glued together via the integral in (5.1). Thus, the non-perturbative
Hilbert space structure of the closed universe with an observer is inherited from that of
the two-sided black hole without an observer.
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Note that although the presence of flavor indices means that, in a sense, there are “more”
null states than in the case without matter, it does not mean that any two states that differ
only in their flavor indices are the same state non-perturbatively. This is due to the fact
that the states |El, Er,∆i⟩ and |El, Er,∆j⟩ for El, Er in the non-perturbative spectrum of
the theory are only the same up to the matter wavefunctions Oi,j(El, Er) in (5.8). Thus,
superpositions of such states over different energies will not be proportional to each other.
This explains how, in section 4.1, we found that a collection of states with varying flavor
index can still span the full non-perturbative Hilbert space. In section 4.1, we worked with
states at fixed temperatures βl = βr but varying flavor index. In that context, we found that
null states only became important with a flavor index number K of at least e2S0 .

Given the null states described above, we then have a non-isometric map, of the type
discussed in [38, 106], connecting the perturbative Hilbert space of a closed universe with an
observer Hrel

pert to the non-perturbative Hilbert space of a closed universe with an observer
Hrel

non-pert. Furthermore, there is yet another map connecting the perturbative Hilbert space
with an observer Hrel

pert to the non-perturbative Hilbert space without one Hnon-pert. In other
words, we get two non-isometric maps

Hrel
pert

VObs.−−−→ Hrel
non-pert,

Hrel
pert

Vno-Obs.−−−−−→ Hnon-pert, (5.16)

where VObs. is implemented by the inner product g∆O
(Hl, Hr) in (5.11) and Vno-Obs. is

implemented by the projector onto the observer’s state |OO⟩⟨OO|lr as in (5.12). An exactly
analogous structure as in (5.16) exists for the case of the two-sided black hole, except in that
case, obviously, the dimensions of Hrel

non-pert and Hnon-pert are different, namely e4S0 and e2S0

respectively. Note that in both cases, we can also find a non-isometric map between Hrel
non-pert

and Hnon-pert. In the context of two-sided black holes, one can consequently use the ideas
of [86] to rewrite operators on Hrel

non-pert as non-linear, state-dependent observables on Hnon-pert.
It would be interesting to work out explicit formulae for such a non-linear reconstruction.

6 Observables along the worldline

We will now analyze the possible observables that act on the Hilbert space Hrel
non-pert that

a gravitating observer can measure. Before that, we should address a basic point. The
evolution of a gravitating observer is, in principle, fully determined through the Wheeler-
deWitt constraint, and the observer cannot make any measurements not determined by
this constraint. The only quantities that we can consequently calculate are the transition
probabilities between the different states of the observer as in section 3. We remark that we
have used an oversimplified model of the observer: in the action (3.1), we have, for instance,
neglected the coupling between the observer’s worldline and other matter fields in the theory.
By computing correlation functions of operators constructed from these fields and dressed
to the worldline of the observer, we can understand what would happen to the observer
in more realistic models and quantify when non-perturbative effects severely modify the
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transition probabilities between different states in Hrel
non-pert ⊗Hobs.35 In the case of a closed

universe, we will see that, in contrast to the global picture, correlation functions of matter
operators dressed to the worldline are not affected by non-perturbative effects, at least far
from the Big Bang and Big Cruch singularities. For two-sided black holes, we will see that
for some observables, such as the length of the Einstein-Rosen bridge seen by an observer
inserted at late times, the global picture and the observer’s point of view agree; in both cases,
non-perturbative effects become important at times t = O(eS0) and cause the length of the
Einstein-Rosen bridge to plateau. For other observables, which capture the experience of an
infalling observer more accurately, the two pictures prove drastically different. For example,
the center-of-mass (CM) collision energy between the observer and a perturbation behind
the horizon of the black hole receives large non-perturbative corrections at times t = O(S0)

— i.e., close to the Page time — in the global picture. On the contrary, the perturbative
calculation of this collision energy proves reliable until times t = O(eS0) when describing
physics from the point-of-view of the observer using our proposal.

6.1 Examples of what an observer sees in a closed universe

To contrast the difference between observables measured in the global Hilbert space and
from the point of view of a gravitating observer, let us compute a correlation function for a
matter field ϕ measured along the observer’s worldline, with the operator insertions dressed
to the state of the clock that the observer carries. For simplicity, we will take this correlation
function to be a two-point function and assume that ϕ interacts with the observer only
gravitationally. As in section 3, we will prepare the state of the observer |β,Ot=0⟩ on the
asymptotic boundary so that the clock reads t = 0 on the smooth closed geodesic slice and
keep track of the time along the worldline with respect to this slice. While the notion of the
clock of the observer only makes sense in Lorentzian signature, for computational purposes
it is useful to first consider the Euclidean two-point function ⟨β,Ot=0|ϕ(τ1)ϕ(τ2) |β,Ot=0⟩.
The relevant geometry is shown in figure 12. We will then analytically continue τ1,2 = −it1,2
to obtain the Lorentzian two-point function.

The global picture. To start, let us briefly discuss the global picture, in which the observer
is treated as an ordinary matter field. In this case, it is impossible to come up with a
well-defined clock for the observer. Because the Hilbert space Hnon-pert is one-dimensional,
the overlap between states defined on spatial slices with the observers’ clocks reading different
times t1 and t2 always has large fluctuations. In fact,

|
〈
β,Ot=t1

∣∣β′, Ot=t2

〉
|2 = 1 (6.1)

if the states are unit-normalized. Similarly, the two-point function when ϕ is inserted at
different times has a large standard-deviation and can only differ by a phase,

| ⟨β,Ot=0|ϕ(t1)ϕ(t2) |β,Ot=0⟩ |2

| ⟨β,Ot=0|ϕ(t′1)ϕ(t′2) |β,Ot=0⟩ |2
= 1 , (6.2)

35Specifically, such correlation functions determine the transition amplitudes when the action (3.1) is
modified by source terms. For example, we can modify the action by coupling a field ϕ(x) that exists
everywhere in the bulk to sources, Isource =

∫
du

√
hj(u)ϕ(u).
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Figure 12. Euclidean diagrams showing the two-point function of a scalar field ϕ, dressed to the
worldline of the observer. The figure on the right is obtained by cutting the figure on the left along
the observer’s worldline, embedding the resulting geometry in the Poincaré disk (depicted in black),
and then identifying the two red geodesics of length ℓ in the right diagram. We give an example of the
worldline connecting the two operator insertions that winds once around the cylinder, which we show
in dark green in both diagrams. The light green circle (left) and line (right) represent the shortest
closed geodesic on the geometry, while the blue line (only shown on the right) is the shortest geodesic
(not closed) perpendicular to the worldline of the observer on both ends. To evaluate the two-point
function in the Lorentzian closed universe we perform the analytic continuation τ1,2 = −it1,2.

regardless of the times t1,2 and t′1,2. This is again because, in the one-dimensional Hilbert
space Hnon-pert, unit-normalized states labeled by any time can only differ from each other
by a phase of the closed universe, and operators can only be multiples of the identity. Of
course, this simply means that physics is trivial. This is not what we expect an observer to
see in a closed universe. To obtain a sensible result, we will recompute the same two-point
function in the same closed universe state following our new proposed rules.

Correlation functions from an observer’s point of view. When computing correlation
functions using the gravitational path integral from an observer’s point of view, the perturba-
tive answer dominates.36 This is again because the disconnected diagrams that connect the
different bras and different kets in the global picture (see section 2.3) no longer contribute
once we impose that the observer’s worldline connects each bra to the corresponding ket.
Since even the perturbative answer is physically interesting in a closed universe, we will
focus on finding the two-point function at leading order in e−S0 , leaving all computations
of non-perturbative corrections for future work.

Before discussing the computation of the two-point function ⟨β,Ot=0|ϕ(τ1)ϕ(τ2) |β,Ot=0⟩,
it will be useful to rewrite the inner-product between two asymptotic states by gluing patches
bounded by geodesic segments whose length is fixed. The Euclidean version of a closed universe
can be decomposed into a quadrilateral with geodesic boundaries — with two opposite sides
that are equal — and two Hartle-Hawking disk wavefunctions, φβ(ℓ); see the right diagram in
figure 12. We will denote the path integral contribution of the quadrilateral by I4(ℓi, ℓ, ℓf , ℓ),
where ℓi and ℓf are the renormalized lengths of the geodesics wrapping the cylinder that

36We believe this happens at least when the observer is not parametrically close (in e−S0 ) to the singularity.
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start and end at the location of the observer insertion at the asymptotic boundary and ℓ is
the renormalized length of the observer’s worldline between the two asymptotic boundaries.
The inner-product between two asymptotic states |β,Ot=0⟩ can then be rewritten as

〈
β,Ot=0

∣∣β′, Ot=0
〉
=
∫
dℓidℓfdℓφβ(ℓi)φβ′(ℓf )e−∆OℓI4(ℓi, ℓ, ℓf , ℓ), (6.3)

where

I4(ℓi, ℓ, ℓf , ℓ) = eS0

∫
dEρ0(E)φE(ℓi)φE(ℓ)φE(ℓ)φE(ℓf ) . (6.4)

In this decomposition of the geometry, it is also useful to note that the distance u between
the two geodesics whose renormalized lengths are ℓ in the quadrilateral, i.e., the length
of the geodesic that wraps the cylinder once and is perpendicular to the worldline of the
observer at both ends, is fixed to be37

sinh2
(
u

2

)
= e

ℓi+ℓf
2 −ℓ . (6.6)

When the observer is heavy (∆O ≫ 1), the relative twist between the observer insertions on
the two asymptotic boundaries is minimized, and the geodesic of length u agrees with the
closed smooth geodesic that wraps the cylinder, whose length we denote by b. In this limit, the
observer enters the Lorentzian spacetime perpendicular to the time-reflection symmetric slice,
and we don’t have to deal with the subtlety of the observer not traveling on a real Lorentzian
path as discussed in section 3. We take this limit, which will, therefore, greatly simplify the
calculation. As mentioned in section 3, when performing the analytic continuation τ → −it
to Lorentzian signature, there is a big bang singularity located at t = −π

2 and a crunch
singularity located at t = π

2 along the worldline of the observer when the observer worldline
is perpendicular to the time-reflection symmetric slice.

To account for the two-operator insertion, we now simply need to compute the lengths of
all possible geodesic connecting the two points where we insert the operators ϕ on the worldline
of the observer. The Euclidean proper times for these points are τ1 and τ2, where τ = 0 is

37This can be computed using the fact that three lengths in a quadrilateral with two right angles determine
the fourth length. We will use this property for two quadrilaterals, one involving the geodesic of length u

and renormalized length ℓi and the other involving the geodesic of length u and renormalized length ℓf (see
figure 12). In the quadrilateral involving the geodesic of length u and the geodesic of proper length ℓ̃i we have,

sinh2
(
ℓ̃i

2

)
= sinh2

(
u

2

)
cosh

(
ℓ̃1
)
cosh

(
ℓ̃2
)
+ sinh2

(
ℓ̃1 − ℓ̃2

2

)
⇒ eℓi ≈ sinh2

(
u

2

)
eℓ1+ℓ2 , (6.5)

where ℓ̃1 and ℓ̃2 are the proper lengths for the side edges of the quadrilateral with two right angles and ℓ1, ℓ2
and ℓ are renormalized lengths. In the quadrilateral involving the geodesic of length u and the geodesic of
length ℓ̃f we have

sinh2
(
ℓ̃f

2

)
= sinh2

(
u

2

)
cosh

(
ℓ̃3
)
cosh

(
ℓ̃4
)
+ sinh2

(
ℓ̃3 − ℓ̃4

2

)
⇒ eℓf ≈ sinh2

(
u

2

)
eℓ3+ℓ4 ,

where, once again, ℓ̃3 and ℓ̃4 are the proper lengths for the side edges of the quadrilateral with two right
angles and ℓ3, ℓ4 and ℓf are renormalized lengths. Here, we have made use of the fact that all proper lengths
diverge in the same way, which lets us ignore the exponential factors of their differences. Using the fact that
ℓ = ℓ3 + ℓ1 = ℓ2 + ℓ4, (6.6) follows.
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fixed to be on the minimal closed geodesic. The shortest such geodesic follows the observer’s
worldline. However, in a closed universe setup, there are additional geodesics connecting the
two points that wrap around the Euclidean cylinder (or, in Lorentzian signature, the closed
universe). In terms of u, the lengths ℓ(n)12 of such geodesics in Euclidean signature are given by38

sinh2
(
ℓ
(n)
12
2

)
= sinh2

(
nu

2

)
cosh(τ1) cosh(τ2) + sinh2

(
τ1 − τ2

2

)
, (6.7)

where n is the number of times that a given geodesic wraps around the universe (with n = 0
corresponding to the shortest geodesic). Analytically continuing to Lorentzian signature
(τ1,2 → −it1,2) we find that the geodesic distances ℓ(n)12 are given by

sinh2
(
ℓ
(n)
12
2

)
= 1

2

(
−1 + 1

ξ
(n)
12

)
, (6.8)

where ξ
(n)
12 are the chordal distances

ξ
(n)
12 = 1

sin(t1) sin(t2) + cosh(nu) cos(t1) cos(t2)
. (6.9)

When the r.h.s. of equation (6.8) is negative and ℓ
(n)
12 is purely imaginary, the geodesic

connecting the two operator insertions is timelike (ξ(n)12 > 1); when it vanishes, the geodesic
is null (ξ(n)12 = 1); when it is positive and ℓ

(n)
12 is purely real, the geodesic is spacelike

(0 ≤ ξ
(n)
12 < 1). If we set the first point at t1 = 0, then the two points become null separated

whenever cos(t2) = 1/ cosh(nu). Thus, the worldline of the observer intersects its own past
lightcone that starts at the t = 0 point. As the crunch singularity (or, similarly, the bang
singularity in the past) is approached, the number of lightcone intersections grows, and
the observer intersects this past lightcone an infinite number of times as they approach the
singularity. This is shown in figure 13. In terms of the chordal distance (6.9), the Wightman
propagator in AdS2 for the field ϕ, with scaling dimension ∆, is given by [107]

G∆(ξ) =
2−∆Γ(∆)

(2∆− 1)π
1
2Γ
(
∆− 1

2

)ξ∆F (∆2 , ∆2 + 1
2;∆ + 1

2; ξ
2
)
. (6.10)

This propagator has a divergence in the coincident point limit or whenever the points become
null-separated. Thus, we expect that the observer will see a divergence in the two-point
function whenever they insert the second operator at a point on the future lightcone of the
first operator insertion. As we have seen, the number of such points — and therefore the
number of divergences — itself diverges as the observer approaches the singularity.

To obtain the Wightman propagator in the fluctuating spacetime, we need to sum the
contribution from all the geodesics that wind around the closed universe and write this
propagator in terms of the geodesic lengths in the quadrilateral with length ℓi, ℓ, ℓ, and ℓf .

38This once again follows from the fact that three lengths in a quadrilateral with two right angles determine
the fourth length — e.g., see (6.5).
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Figure 13. Two frontal views of the closed universe in Lorentzian signature. The observer’s worldline
is depicted in red and the maximal Cauchy slice of length b is depicted in green. We insert a matter
insertion at time t1 = 0, defined by where the observer intersects this Cauchy slice. Another matter
insertion is place sometime later along the observer’s worldline. (Left) Left and right null rays
emanating from the first matter insertion are shown in brown. Each time the second operator insertion
is placed at the intersection of these null rays with the worldline of the observer, the two-point function
on a fixed background diverges. (Right) Generically, an infinite number of winding geodesics contribute
to the two-point function. A timelike geodesic along the observer’s worldline is drawn in purple, a
winding spacelike geodesic is drawn in blue, and a null winding geodesic is shown in brown.

The resulting (un-normalized) Wightman propagator is given by

⟨β,Ot=0|ϕ(t1)ϕ(t2) |β,Ot=0⟩ =
∞∑

n=−∞

∫
dℓidℓfdℓφβ(ℓi)φβ′(ℓf )e−∆OℓI4(ℓi, ℓ, ℓf , ℓ)G∆(ξ

(n)
12 ),

(6.11)

where ξ(n)12 is given by equation (6.9) with u given by equation (6.6). Because the propagator
has only a mild logarithmic divergence when the points of the two operator insertions become
null separated (i.e., when ξ

(n)
12 → 1), this divergence is smoothed out by the fluctuation in

the lengths ℓ, ℓi and ℓf that are captured by the integral in equation (6.11). Thus, the
two-point function of ϕ becomes well defined along the entire worldline of the observer due
to quantum gravity fluctuations. While this might be a desirable feature, we do not see a
contradiction with such divergences appearing when computing observables in the Hilbert
space of closed universes. This is because even though the Hilbert space we computed in
section 4.1 was finite, there, we restricted to asymptotic boundaries whose ADM energy
(labeled by E = s2/2) was within a given energy window that could be arbitrarily large
but finite. When acting with the operator ϕ on a time slice, the resulting state might have
support outside of the space spanned by the states specified by the asymptotic boundary
condition whose ADM energy is within a finite window. In fact, we can explicitly see that
more serious divergences (for example, those appearing in the two-point function of ∂k

t ϕ(t)
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for k > 1) persist even after performing the integral over metric fluctuations.39 Interestingly,
the accumulation of such divergences provides a way to probe the crunch singularity of the
closed universe. Even more interestingly, when probing this accumulation of divergences, the
relevant Euclidean geodesic in the calculation of the propagator (6.11) winds a very large
number of times around the closed universe and has an arbitrarily long length, nu. Typically,
the appearance of such long geodesics — such as the long geodesics probing the length of
the Einstein-Rosen bridge at times t ∼ eS0 that we shall analyze in the next subsection —
signals the fact that non-perturbative effects become important and could drastically alter
the perturbative calculation presented above. It would be interesting to perform such a
non-perturbative analysis in future work.

6.2 Examples of what an observer sees when falling into a black hole (I):
the length of an ER bridge

Our computation of correlators dressed to the worldline of the observer can easily be
generalized for observers probing two-sided black hole states. However, for two-sided black
holes, such observables are less interesting than their closed universe analog: the winding
geodesics discussed in section 6.1 that appear even at the perturbative level are absent in
the two-sided black hole setting. We do expect non-perturbative corrections to affect such
correlators even for two-sided black holes when the time separation between operator insertions
along the worldline of the observer becomes very large. While in JT gravity such large time
separations are possible, for realistic black holes we expect the observer to hit the black hole
singularity after a finite proper time, making such large time separations impossible. Instead,
for two-sided black holes, we will discuss two other observables — how the length of the
Einstein-Rosen bridge changes with time (in this subsection) and the center-of-mass collision
energy between the observer and an arbitrary matter perturbation coming from the opposite
side (in section 6.3) — that probe what happens to the observer after they pass the horizon.

Following the work of [93, 108, 109], we ask what happens to an observer who jumps into
one side (say the right side) of a two-sided black hole. Unless the black hole was perfectly in
the unperturbed thermofield double state, there will be matter excitations that may have
fallen into the other side of the black hole.40 For simplicity, we will model all the matter
excitations on the left as a single operator insertion on top of the thermofield double. As
illustrated in figure 14, if both the observer and matter fall in at early times, then there will
be a large relative blueshift between the two, which leads to a very high collision energy. On
the other hand, if they fall in at late times, this relative blueshift becomes a redshift, and
the observer feels very little. In [37, 93], it was pointed out that a gauge invariant way of
measuring blueshift/redshift is to compute the change in time of the length ℓ of the geodesic
slice connecting the observer and matter particle, denoted by p = ℓ̇. If p < 0, the system
is in the so-called “white hole” phase, and the observer and excitation collide with high
energy. If p > 0, the system is in the “black hole” phase, and there is no collision. In [37],

39One can cure such divergences by smearing the insertions of ϕ along (or in the neighborhood of) the
worldline. We also expect such a smearing to decrease the contributions of intermediate states (in between the
two operator insertions) that have large energies, providing an explanation for why such divergences are cured.

40There may also have been excitations which fell in on the side of the observer, but for simplicity, we
restrict ourselves to the situation where all excitations other than the observer fall in from the left.
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WH shrinking
V O

ouch!

WH growing
V O

≃ V

O

Figure 14. The left-most diagram illustrates how if the observer and particle jump in both at early
times, the geodesic slice for the wormhole is shrinking. This leads to a large relative boost between
the observer and the particle and a correspondingly high energy collision. If both insertions happen
far in the future (center diagram), then the observer and particle experience a growing wormhole
length and only a minor collision. In the right-most diagram, we illustrate how the boost symmetry of
the thermofield double can be used to move one of the insertions down to T = 0. In this work we
choose to fix V at T = 0 on the left and vary the time that the observer jumps in. The above figure is
reproduced from figure 1 of [38].

it was observed that non-perturbative wormhole effects could cause a black hole to tunnel
into a white hole at very late times. Thus, even though semiclassically an observer jumping
into a very old black hole would expect to see no collision, a non-perturbative, quantum
tunneling could lead the observer to see one.

In [37–39], the length of the geodesic slice and its time dependence were computed in
various ways, and non-perturbative effects were taken into account. Since p(t) and ℓ(t) are just
properties of the geodesic slice, these computations can be done in pure JT gravity without
matter. When non-perturbative effects are present, there may be more than one geodesic
connecting the same two boundary points — a phenomenon that does not occur at disk level
in JT gravity. There is, therefore, a non-perturbative ambiguity about which geodesic slice is
used to compute ℓ(t). In [37], a proposal was made for how to identify a unique geodesic slice
whose properties could be analyzed, but it was not clear whether this proposal corresponded to
a linear operator (on any Hilbert space), and so it was not clear how to compute probabilities
in a principled manner. In [38], an alternate proposal was made for an infinite family of
length operators, which all act linearly on the non-perturbative Hilbert space of the two-sided
black hole, Hnon-pert, and agree with the disk-level predictions for the length operator.

We now ask how the computations of [38] get modified in the presence of an observer.
Namely, we want to investigate length operators which act linearly on Hrel

non-pert. Note
that such operators can not correspond to linear operators on Hnon-pert, in agreement with
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arguments that observers measure non-linear operators on the boundary Hilbert space [90, 92].
We can start with a disk-level computation. To compute how the length of the geodesic
slice connecting two boundary times changes in the presence of an observer, we want to
compute the diagram

⟨OO(T )| ℓ̂AB |OO(T )⟩ = (6.12)

where we keep in mind that all inner products are computed in Hrel
pert. Here, we insert the

observer at Lorentzian time T and smear its insertion by ε in Euclidean time to make the state
normalizable. Since at the disk-level the observer worldline cannot connect with any other
operators, the diagram in (6.12) could be viewed as a calculation in either Hpert or Hrel

pert.
This diagram can be computed by decomposing the disk into two triangular patches

bounded by geodesics, with the observer’s geodesic ℓO common to both. These triangles
have vertices at A, Oi, Of and B, Oi, Of in the figure in equation (6.12). Sewing along
ℓO with the weighting e−∆OℓO , we find41

⟨OO(T )| ℓ̂AB |OO(T )⟩ =
eS0

⟨OO,
β
2 − iT, ϵ|OO,

β
2 + iT, ϵ⟩

∫
dsi1dsi2dsf1dsf2 ρ0(si1) . . . ρ0(sf2)

×
∫
dℓOdℓAOidℓAOf

dℓBOidℓBOf
ℓAB e−∆OℓOI3(ℓAOi , ℓAOf

, ℓO)I3(ℓBOi , ℓBOf
, ℓO)

× φ̃si1(ℓAOi)φ̃sf1(ℓAOf
)φ̃si2(ℓOiB)φ̃sf2(ℓOf B)e−ε

s2
i2
2 −ε

s2
f2
2 −(β/2+iT )

s2
i1
2 −(β/2−iT )

s2
f1
2 (6.13)

where ℓAB is a function of all five lengths in the problem ℓAB = ℓAB

(
ℓO, ℓAOi , ℓAOf

, ℓBOi , ℓBOf

)
.

The factors of I3 correspond to the path integral of JT gravity over triangular regions of
the hyperbolic disk

I3(ℓ1, ℓ2, ℓ3) =

ℓ1

ℓ2ℓ3 = eS0

∫
dEρ0(E) φ̃s(ℓ1)φ̃s(ℓ2)φ̃s(ℓ3), (6.14)

where in the last equality, we used the results of [98]. We remind the reader that the parameter
ε is present to “smear” the state of the observer so that it is normalizable. In the limit
of small ε, the ℓ-integrals are dominated by very large, negative ℓBOi , ℓBOf

and ℓO. The
41Notice that here we normalize the state for convenience.
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integrals over these three lengths then decouple from the remaining ℓAOi and ℓAOf
integrals.

Furthermore, in the limit of very negative ℓO, I3(ℓAOi , ℓAOf
, ℓO) ∼ δ(ℓAOi − ℓAOf

) up to
order one constants which are canceled by the normalization ⟨OO,

β
2 − iT, ϵ|OO,

β
2 + iT, ϵ⟩.

Additionally, in the small ε limit ℓAOi ≈ ℓAB, and so all-in-all we get

⟨OO(T )| ℓ̂AB |OO(T )⟩ ≈
eS0

Z(β)

∫
dsidsf ρ0(si)ρ0(sf )

(∫
dℓAB ℓAB φ̃si(ℓAB)φ̃sf

(ℓAB)
)

× e−(β/2+iT )Ei−(β/2−iT )Ef . (6.15)

Since ε controls how far away from the black hole the observer jumps from, in the ε → 0
limit, we see that the presence of the observer does not change the expectation value
⟨OO(T )| ℓ̂AB |OO(T )⟩ to leading order in ε. Thus, the disk-level answer for the growth of the
geodesic slice’s length is approximately unchanged relative to what was found in [38]. Indeed,
this simplification actually occurs to all orders in the genus expansion. The only modification
to equation (6.15) when including higher genus corrections is to replace ρ0(si)ρ0(sf ) with the
non-perturbative correlator ρ0(si)ρ0(sf ). In other words, the only higher genus effects that
are important at leading order in ε come from wormholes connecting the two patches in the
figure of (6.12) that are bounded by T -dependent boundary lengths. Thus, at least when
the observer jumps in very far from the black hole (when ε is small), the calculation of the
growth of the length reduces to that discussed in [38] to all orders in the genus expansion.
It would be interesting to analyze such non-perturbative effects when ε is not so small, but
we leave this analysis for future work.

6.3 Examples of what an observer sees when falling into a black hole (II):
collision energy with a shockwave past the horizon

In [38], the authors studied non-perturbative corrections to the center-of-mass (CoM) energy
of the collision between the matter particle, inserted on the left, and the observer, inserted on
the right. The collision energy is a natural observable since it can be measured locally by the
observer — by simply measuring the components of the stress tensor along their worldline —
as opposed to the change in length of the geodesic slice which cannot. Furthermore, it was
shown in [38] that statistics of the CoM energy can be computed analytically by studying
the distribution of Casimir energies of the matter-plus-observer state. The definition of the
Casimir energy will be reviewed shortly. Surprisingly, even though this is a low complexity
observable, the authors found that the non-perturbative corrections became important for
this observable at times that are polynomial in the entropy of the black hole as opposed to
exponential in the entropy. The calculations in [38] seemed to suggest that the notion of an
observer can cease to make sense at times much earlier than exponential in the black hole
entropy, and so EFT can break down at times of order the Page time. In this section, we
revisit the CoM observable and modify it to be an operator acting on the relational Hilbert
space Hrel

non-pert. First, we review the discussion of [38].
The observable discussed in [38] was the center-of-mass energy of a collision experienced

by an observer falling into one side of a black hole in the thermofield double state when
a particle has been dropped into the black hole on the other side. We return now to this
observable, but compute what the observer experiences using our new rules for the inner
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product on the non-perturbative relational Hilbert space. Consider the state |VOO(−T )⟩,
where V is inserted on the left at boundary time t = 0 and OO on the right at boundary time
t = −T . Perturbatively, we can understand the resulting state as living in the Hilbert space
of JT gravity with matter [38, 96, 97]. As we reviewed in section 2, the matter states can be
organized into representations of the background SL(2,R) symmetry, with ordinary matter
falling into discrete series representations. These representations are labeled by a Casimir
value C∆ related to the mass/dimension ∆ of the field via C∆ = ∆(∆ − 1).

When two operators labeled by masses ∆O and ∆V are inserted at the boundary, the full
bulk state, including the perturbative gravitational fluctuations, can then be expanded as a
superposition over different representations by using “gravitationally-dressed blocks” [102].
The operator that measures the SL(2, R) Casimir in each representation appearing in this
expansion can be directly related to the operator which measures the center-of-mass collision
energy experienced by the two particles [38]. By measuring the Casimir, we are measuring
the collision energy experienced by the observer.

We now explain these words in more detail. In [38, 102], the gravitationally-dressed
blocks can be represented by the diagram

P∆V ,∆O
n (s; sL, sR) = sL sR

s∆V ∆O

∆V +∆O + n

, (6.16)

where the observer and particle have masses ∆O and ∆V respectively. Like in previous
sections, the s-labels are related to the energy of the boundary particle in that region by
E = s2/2. The resulting Casimir value, Cn, after fusing these two operators is that of a
particle with mass ∆n = ∆V + ∆O + n, namely Cn = ∆n(∆n − 1). Furthermore, these
blocks obey an orthogonality relation42∫

ds ρ0(s)P∆V ,∆O
n (s; sL, sR)P∆V ,∆O

m (s; sL, sR) = δnm (6.17)

and a completeness relation

δ(s− s′)
ρ0(s)

=
∞∑

n=0
P∆V ,∆O

n (s; sL, sR)P∆V ,∆O
n (s′; sL, sR). (6.18)

This completeness relation can be summarized in the following schematic [102]

∆V ∆O

∆V ∆O

sL sR

s

s′

1 =
∞∑

n=0
sL sR

s

s′

∆V ∆O

∆V ∆O

n (6.19)

42Note that due to a factor of 2 difference between ρ0 in this work compared to [102], our P∆V ,∆O
n ’s differ

by a factor of
√
2 from [102] so that equation (6.17) still holds.
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Using these relations, we can define states of definite Casimir by integrating over states
defined by asymptotic boundary conditions as43

|n, sL, sR⟩LR = e−S0/2
∫
ds ρ0(s)

Pn(s; sL, sR)√
γ∆V

(sL, s)γ∆O
(sR, s)

|sL, sR, VOOs⟩LR (6.20)

where the normalization factors γ are given in equation (2.24). By construction, the eigenvalue
of the state |n, sL, sR⟩ under the Casimir operator Ĉ is given by Ĉ |n, sL, sR⟩ = Cn |n, sL, sR⟩.
The state |sL, sR, VOOs⟩LR is a bulk state defined by asymptotic boundary conditions,
pictorially represented as

|sL, sR, VOOs⟩LR =

OOV

s
sL sR

. (6.21)

From this definition, we have

LR

〈
sL,sR,VOOs

∣∣s′L,s′R,VOOs
′〉

LR = eS0 δ(sL−s′L)δ(sR−s′R)δ(s−s′)
ρ0(sL)ρ0(sR)ρ0(s)

γ∆V
(sL,s)γ∆O

(sR,s)

(6.22)

Therefore, the norm of the states in (6.20) is44

〈
n, sL, sR

∣∣m, s′L, s′R〉 = δ(sL − s′L)δ(sR − s′R)
ρ0(sL)ρ0(sR)

×
∫
dsds′ρ0(s)ρ0(s′)Pn(s; sL, sR)Pm(s′; sL, sR)

δ(s− s′)
ρ0(s′)

= δnmδ(sL − s′L)δ(sR − s′R)
ρ0(sL)ρ0(sR)

, (6.23)

where we used (6.17). We then see that the |n, sL, sR⟩ states are also plane-wave normalizable,
and form a complete basis of states in which we can expand a given state. To make these
normalizable in the standard sense, we should imagine integrating sL and sR over a small
window of size δs centered around sL,R. To normalize the states we divide by

√
ρ0(s)δs

so that the normalized states are

|n, sL, sR⟩ =
∫ sL,R+δs/2

sL,R−δs/2
dsLdsR

ρ0(sL)ρ0(sR)
δs
√
ρ0(sL)ρ0(sR)

|n, sL, sR⟩ . (6.24)

We will often leave this smearing over sL and sR implicit below unless necessary.

43From this equation forward, we will often drop the super-script ∆V ,∆O on the gravitational-blocks
P∆V ,∆O

n ’s since we will always be considering the same two operators, V and OO.
44The states |n, sL, sR⟩ are the same (up to a normalization constant) as the states |∆, EL, ER⟩ introduced

in equation (2.23), where ∆ = Cn.
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Perturbative probability of detecting a fixed Casimir. To understand the distribution
of collision energies discussed in [38], we would like to expand the state with an observer
inserted at Lorentzian boundary time t = −T in the past on the right and a particle inserted
at boundary time t = 0 on the left, denoted |V (0)OO(−T )⟩ in the basis of Casimir states we
just introduced. To make the state |V (0)OO(−T )⟩ normalizable we move the two operators
off the τ = 0 slice in Euclidean time by an amount ε. The overlap between the two states is〈

n, sL, sR

∣∣∣V (0)OO(−T )
〉

= e−S0/2
∫
dsρ0(s)

Pn(s; sL, sR)√
γ∆V

(sL, s)γ∆O
(sR, s)

⟨sL, sR, VOOs|V (0)OO(−T )⟩
(6.25)

At the disk level, the inner product inside the integral is just〈
sL, sR, VOOs

∣∣∣V (0)OO(−T )
〉

= eS0e−
εs2

L
2 −

εs2
R
2 −(β/2−iT ) s2

2 ×
√
γ∆V

(sL, s)γ∆V
(sL, s)γ∆O

(sR, s)γ∆O
(sR, s)

(6.26)

and so〈
n, sL, sR

∣∣∣V (0)OO(−T )
〉

= eS0/2
∫
dsρ0(s)Pn(s; sL, sR)e−

εs2
L
2 −

εs2
R
2 −(β/2−iT ) s2

2 ×
√
γ∆V

(sL, s)γ∆O
(sR, s).

(6.27)

With these overlaps in hand, we can then compute the expectation value in the |VOO⟩ state
of the projector onto a fixed n eigenspace

Πn ≡
∫
dsLdsR ρ0(sL)ρ0(sR) |n, sL, sR⟩⟨n, sL, sR| (6.28)

We thus get that the distribution of n-eigenvalues takes the form

p(n) = eS0

⟨VOO|VOO⟩

∫ ∞

0

4∏
j=1

(
dsjρ0(sj)e−τj

s2
j
2

)

× [γ∆V
(s1, s2)γ∆O

(s2, s3)γ∆O
(s3, s4)γ∆V

(s4, s1)]1/2 P∆V ∆O
n (s4; s1, s3)P∆V ∆O

n (s2; s1, s3),
(6.29)

where here {τ1, τ2, τ3, τ4} = {2ε, β/2 − iT, 2ε, β/2 + iT} and s1 = sL, s3 = sR, s2 = s

and s4 = s′. This is the Casimir distribution quoted in [38]. By using equation (6.18)
together with the fact that

⟨VOO|VOO⟩ = eS0

∫ ∞

0

3∏
j=1

(
dsjρ0(sj)e−τj

s2
j
2

)
γ∆V

(s1, s2)γ∆O
(s2, s3),

{τ1, τ2, τ3} = {2ε, β, 2ε}, (6.30)

we see that this distribution is normalized in n.
Without Schwarzian, gravitational effects, this distribution is sharply peaked for early

times about n ∼
√
∆V ∆Oe

πT/β.45 Thus, the collision energy experienced by the observer
45For an explanation of this point, see Section 7.2 of [38].
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grows exponentially. To understand gravitational effects, it is then warranted to expand
the gravitational blocks above at large n. As explained in appendix B of [38], at large n
the blocks Pn(s; sL, sR) take the form

Pn(s; sL, sR)

=

√
4Γ(∆V ± isL ± is)Γ(∆O ± isR ± is)

n

(
Γ(2is)e2is logn

Γ(∆V ± isL + is)Γ(∆O ± isR + is) + c.c.

)
.

(6.31)

Furthermore, at large ∆V /ε and ∆O/ε, it is natural to work with re-scaled variables s1,3 =
∆V,O/εσ1,3 in the integral in (6.29). Expanding the Gamma-functions in (6.31) at large
∆V,O/ε and plugging the result into (6.29), we can then perform the σ1 and σ3 integrals
by saddle point, and indeed one finds saddle point values at σ1,3 ∼ O(1). Furthermore,
in this limit, the σ1,3 integrals decouple from the s2, s4 integrals in (6.29), and, to leading
order in ∆/ε, the σ1,3 integrals just give a factor of ⟨VOO|VOO⟩ /Z(β) with ⟨VOO|VOO⟩
evaluated in the ∆/ε → ∞ limit of (6.30).

When the dust settles, one finds that the full normalized distribution in (6.29) is [38]

p(n) = 4
nZ(β)

∫ ∞

−∞
ds2ds4ρ0(s2)ρ0(s4) exp

(
−β4 (s

2
2 + s24) + i

T

2 (s
2
2 − s24)

)
× Γ(2is4)Γ(−2is2) exp

(
i2(s2 − s4) log

n

4∆
ε

)
+O(ε/(∆)). (6.32)

Finally changing to sum and difference variables, s± = s2 ± s4, we see that the integral is
dominated by s− ≪ s+. The resulting integral becomes a sharply peaked Gaussian in log n/n0
with mean ∼ πT/β and width growing linearly in T . Changing from n to Cn ∼ n2 variables,
where Cn is the eigenvalue under Ĉ, one finds the Casimir distribution quoted in [38]

p(C) =
β3/2Φ

1
2
b log C

C0

C
√
8π3T 2

exp
(
−βΦb

2T 2

(
log C

C0
− 2πT/β

)2
)
, (6.33)

where C0 = 16∆2Φ2
b

ε2 . Here we reintroduced the Schwarzian coupling Φb, with Φb ≫ β, T in
the semiclassical limit which we are interested in. Integrating over C, one can check that
this distribution is indeed normalized. The important point about this distribution is just
that near the peak at C ∼ C0e

2πT/β,46 the distribution has a height which is exponentially
decaying in time, due to the factor of 1/C in front of the Gaussian. In other words, at times
of order S0, the distribution is dominated by values which are exponentially small in the
entropy and so are susceptible to e−S0-suppressed corrections. We turn now to discussing
such non-perturbative corrections and how they are suppressed in the presence of an observer.

Wormhole corrections to the CM collision energy: the global picture. So far,
we have computed the disk-level/semi-classical contribution to the distribution of Casimir

46The distribution (6.33) is only valid for C ≫ 1, C ≫ C0. The peak is at C ∼ C0e
2πT/β only in the

semiclassical limit γ ≫ β, T .
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energies in the state |V (0)OO(−T )⟩. This can be visualized as computing the contribution
to the gravitational path integral from the spacetime

β + it

β − it

Πn

Oi

Of

V

V
, (6.34)

where we have inserted the projector onto fixed n states, Πn, defined in (6.28). Now we would
like to compute the contribution from higher genus wormholes. The contribution we will be
most interested in is when the projector, Πn, “threads” the wormhole as follows:47

P2

V

V

O

O

Πn

. (6.35)

Now by equation (6.28), computing the expectation value of Πn requires us to compute
the square of ⟨n, sL, sR|V (0)OO(−T )⟩. Accordingly, we can cut the wormhole in (6.35) along
the dashed line and view it as a bra-ket to bra-ket wormhole between the two copies of
⟨n, sL, sR|V (0)OO(−T )⟩ in the expectation value of Πn. Via the definition of the states
in (6.20), we can then replace the |n, sL, sR⟩ states with an integral over s of |sL, sR, VOOs⟩
states. In this way, we can view the wormhole in (6.35) as (an integral of) the cylinder
between two asymptotic boundaries. These two steps of cutting the wormhole in (6.35) and
then replacing |n, sL, sR⟩ boundaries with asymptotic boundaries are depicted in figure 15.48

We can then compute the two-boundary wormhole in figure 15 by summing over different
contractions of the various boundary operators. Without any restrictions on which contractions
we sum over, the dominant contraction will be the one where each operator pairs up with
its corresponding operator on the opposite boundary. Since the two-boundary wormhole
can be constructed by doing an identification of global AdS2, the relevant contraction can

47One can check that contributions in which the projector does not thread the wormhole are exponentially
suppressed in S0 and have the same 1/n-suppression as the perturbative result.

48Note that the factor of e−S0/2 in (6.25) accounts for the eS0 difference between the geometry in (6.35)
(genus one) and the geometries in figure 15 (genus zero).
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Figure 15. The left figure illustrates the geometry obtained upon cutting the wormhole in (6.35) along
the dashed line. The resulting geometry corresponds to the bra-ket to bra-ket wormhole contributing
to the square of ⟨n, sL, sR|V (0)OO(−T )⟩. In the right figure, the |n, sL, sR⟩ boundary conditions are
replaced by (an integral of) asymptotic boundary segments given by the state |sL, sR, VOOs⟩.

be visualized as a diagram on global AdS2 as

sL

sL

sR

sR

β/2 + iT

β/2− iT

s

s′

= =

V V OO OO

V V OO OO

= .

(6.36)

From now on, below, we will directly draw the diagram on the right that schematically shows
the operator contraction. Such diagrams can be computed using standard rules derived
in [102]. The rules state that for each intersection of a matter/observer worldline with an
asymptotic boundary particle worldline, the diagram receives a

√
γ∆(s1, s2) vertex factor.

Furthermore, asymptotic boundary regions that are shaded the same color share the same
energy or s-variable. Putting these rules together, this diagram gives∫

dλ ρ0(λ) e−ε(s2L+s2R)−β λ2
2

√
γ∆V

(sL, s)γ∆O
(sR, s)γ∆V

(sL, s′)γ∆O
(sR, s′)

× γ∆V
(sL, λ)γ∆O

(sR, λ)
δ(s− s′)
ρ0(s)

. (6.37)

Integrating this expression against Pn(s) and Pn(s′) to project onto fixed Casimir states
as in (6.20), we see that the γ factors inside the square-root in (6.37) cancel against those
in (6.20). Plugging into (6.20) and using the orthogonality relations for the Pn’s in (6.17) gives

| ⟨n, sL, sR|VL(0)OO(−T )⟩ |2 ⊃ e−S0

∫
dλ ρ0(λ) e−ε(s2L+s2R)−β λ2

2 γ∆V
(sL, λ)γ∆O

(sR, λ). (6.38)
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To compute the contribution of this overlap to the probability distribution in n, we need to
compute the expectation value of the projector in (6.28), which involves integrating (6.38)
over sL, sR. Doing so, we see that (6.38) just contributes an amount equal to the norm of
the state |VL(0)OO(−T )⟩ given in (6.30) up to a factor of e−2S0 . Dividing (the integral over
sL, sR of) (6.38) by the norm of the state (6.30) to compare with the disk distribution, we
arrive at a wormhole contribution to the probability distribution p(n) which is n-independent
but suppressed by an amount e−2S0 . At the peak of the distribution in (6.33), this wormhole
correction will become dominant at times T/β of order S0. Note that such a correction, in fact,
leads to a non-normalizable distribution for n (or the Casimir). This is just reflective of the fact
that the |n, sL, sR⟩ states are over-complete with respect to the non-perturbative inner product.

Wormhole corrections to the CM collision energy: the observer’s point of view.
We will now discuss how this effect is eliminated when using our modified inner product in
the presence of an observer. Using our rules for the quantum gravity relational Hilbert space,
we should always contract the operator OO with a partner in the same bra-ket pair. In other
words, when using the non-perturbative inner product in the presence of an observer, the
observer’s worldline should never cross the wormhole. This property disturbs the contraction
that led to the factor of δ(s− s′) in (6.37). For other matter particle contractions, the use of
the orthogonality relation gets spoiled, leaving behind Pn’s, which are suppressed by factors
of 1/

√
n due to (6.31). This means that the wormhole corrections in the non-perturbative

observer Hilbert space are of the same order in n-counting as the perturbative answer (6.33),
but they are suppressed in eS0-counting.

We now explain these words in more detail by examining the form of other contractions
and how they contribute to | ⟨n, sL, sR|V (0)OO(−T )⟩ |2. In our modified inner product rules,
the observer operator inside the definition of the state |n, sL, sR⟩ in (6.20) will always connect
with the observer operator in the corresponding bra/ket. Assuming that no particle worldlines
cross (as we have done throughout this work), we are just left with two classes of diagrams,
depending upon whether the worldline of VL traverses the wormhole or not.49 For the
class of diagrams where the VL operator’s worldline crosses the wormhole, there are two
possible contractions which we need to evaluate to compute | ⟨n, sL, sR|V (0)OO(−T )⟩ |2. The
important contractions can be illustrated as

sL

sL

sR

sR

β/2 + iT

β/2− iT

s

s′

= =

V V OO OO

V V OO OO

+

sL

sL

sR

sR

β/2 + iT

β/2− iT

s

s′

= =

V V OO OO

V V OO OO

. (6.39)

49We are focusing here again on diagrams for which the projector threads the wormhole. We will find that
these diagrams are suppressed by 1/C and eS0 ; we remark that diagrams in which the projector does not
thread the wormhole are also suppressed by 1/C and eS0 and therefore give corrections to the perturbative
answer at the same order. However, unlike one of the diagrams we will compute, they are time-independent
and will therefore not be enhanced at exponential times.
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As in (6.37), to get to the overlap | ⟨n, sL, sR|V (0)OO(−T )⟩ |2, we need to integrate these
diagrams over s, s′ against the kernel in (6.20). Again following the Feynman diagram-like rules
discussed in [102] for computing the contribution of such spacetimes, the left diagram gives

|⟨n,sL,sR|V (0)OO(−T )⟩|2⊃e−S0

∫
ds ρ0(s)e−ε(s2L+s2R)−β s2

2 γ∆V
(sL,s)γ∆O

(sR,s)P 2
n(s,sL,sR).

(6.40)

The time dependence of this contribution has canceled out because the two asymptotic regions
whose length depends on T share the same energy variable s. Importantly, the presence of
the Boltzmann factor has spoiled the enhancement in the integral over s that the diagram
computed in (6.38) exhibited. One way to see that the enhancement is gone is that in the
calculation that leads to equation (6.38), the piece of the s-integral that scales as n comes
from the large s region, where the integrand oscillates sinusoidally. In (6.40), the large-s
region of the integral is damped by the factor of e−βs2 , which was not present in the s-integral
in (6.37). The second diagram gives

| ⟨n, sL, sR|V (0)OO(−T )⟩ |2 ⊃ e−S0e−ε(s2L+s2R)−β
s2

L
2 γ∆V

(sL, sL)γ∆O
(sR, sL)P 2

n(sL; sL, sR),
(6.41)

where the s and s′ integrals have been localized to s, s′ = sL. Again, this diagram is
time-independent and decays like 1/n at large n from the factors of Pn(sL; sL, sR).

In the second class of diagrams, the matter operator V does not traverse the wormhole.
Now, there are three diagrams to consider, which look like

sL

sL

sR

sR

β/2 + iT

β/2− iT

s

s′

= =

V V OO OO

V V OO OO

+

sL

sL

sR

sR

β/2 + iT

β/2− iT

s

s′

= =

V V OO OO

V V OO OO

+

sL

sL

sR

sR

β/2 + iT

β/2− iT

s

s′

= =

V V OO OO

V V OO OO

(6.42)

These diagrams are a bit more subtle due to the issue that we need to mod-out by the
action of the mapping-class-group (MCG) on the geometry. When matter geodesics traversed
the wormhole, geometries related by MCG transformations were really different since the
traversing geodesic could be used to distinguish the two geometries by measuring its winding
number. Without such a geodesic, MCG transformations are pure gauge. The effect of
doing this quotient by the MCG is just to insert a factor of the density-density correlator,
ρ(s)ρ(s′)conn., into the calculations. This connected piece of the density-density correlator
can be computed in JT gravity to be [13]50

ρ(s)ρ(s′)conn. =
−1
π2

s2 + s′2

(s2 − s′2)2 . (6.43)

50Notice that the connected correlator is between the full densities of states ρ(s) = eS0ρ0(s), and the
connected part of the correlator is O(1) [13, 104].
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Therefore, after inserting (6.42) into the square of (6.25), the first term gives

e−S0

∫
dsds′e−ε(s2L+s2R)−(β/2+iT ) s2

2 −(β/2−iT ) s′2
2

× ρ(s)ρ(s′)conn.Pn(s; sL, sR)Pn(s′; sL, sR)
√
γ∆V

(sL, s)γ∆V
(sL, s′)γ∆O

(sR, s)γ∆O
(sR, s′).

(6.44)

As before, it is convenient to go to s± = s ± s′ variables. The connected correlator of ρ’s
in (6.43) has a double pole at s− = 0 and so, at large T , this integral is dominated by the
s− = 0 region. Again, however, the presence of the Boltzmann factors spoils the enhancement
coming from the large s+ region, and so at large n, this diagram goes like 1/n. Furthermore,
after insertion into the square of (6.25), the second diagram in (6.42) gives

e−S0

∫
dsds′e−ε(s2L+s2R)−(β/2+iT ) s2

2 −(β/2−iT ) s′2
2

× ρ(sR)ρ(sR)conn.Pn(s; sL, sR)Pn(s′; sL, sR)
√
γ∆V

(sL, s)γ∆V
(sL, s′)γ∆O

(sR, s)γ∆O
(sR, s′).

(6.45)

Naively this looks divergent since we are evaluating (ρ(s)ρ(s′))conn. directly on its double pole,
but we should remember that we defined our |n, sL, sR⟩ states to involve a smearing over
sL and sR as in (6.24) so that |n, sL, sR⟩ is normalizable. The effect of this smearing over
sL is just to replace ρ(s)ρ(s′)conn. with a factor of 1/δs. As long as δs is not exponentially
small in S0, again, this term will be suppressed by both e−2S0 and 1/n relative to the leading
perturbative answer in (6.33) once we account for the normalization of the state |VOO⟩.
Finally, this same analysis for the second diagram in (6.42) applies directly to the third
diagram in (6.42) but with ρ(s)ρ(s′)conn. evaluated at s = s′ = sR.

In summary, when using the inner product in the presence of an observer, all genus-one
corrections — such as (6.35) — to | ⟨n, sL, sR|V (0)OO(−T )⟩ |2 are suppressed at large n by
1/n like the disk answer, and they are further suppressed by e−S0 relative to the disk answer.
One could also wonder about higher-genus contributions to these observables. For example,
in the various diagrams of (6.39) and (6.42), we could consider geometries with handles
connecting the various regions of different or the same color. The essential point is that the
large s behavior in all of these diagrams will be damped by the same Boltzmann factors,
so the large n behavior will always be 1/n. Therefore, the higher-genus contributions are
even more suppressed than the geometries studied above.

The upshot of our analysis is then that the probability distribution in the presence of
the observer does not get corrected at times of order S0. Note, however, that there are
contributions to the probability distribution which are exponentially suppressed in S0 and
suppressed in 1/n but have non-trivial time dependence. For example, the first contraction
in (6.42) has non-trivial time-dependence as exhibited in (6.44). At large enough time, this
term gets a contribution that grows linearly in T . This is just the same linear growth in
time exhibited by the spectral form factor. In other words, we expect that the Casimir
distribution, defined using the inner product in the presence of an observer, agrees with
the perturbative answer in (6.33) until times of order eS0 . Therefore, at exponential times,
non-perturbative corrections to the collision energy experienced by an observer become
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important, and perturbative effective field theory breaks down. We remark that this result is
substantially different from the puzzling results of [38], in which effective field theory breaks
down at linear times, namely around the Page time.

7 Discussion

In this paper, we have proposed a modification of the rules of the non-perturbative gravitational
path integral to take into account the presence of a gravitating observer. In our proposal,
we require the observer to always be present on any spatial slice when computing overlaps
between quantum gravity states and their moments. Specifically, a worldline for the observer
must always connect a bra and the corresponding ket. These rules should be applied when
asking questions about the experience of the gravitating observer.

Using our new proposal in the context of two-dimensional JT gravity with a negative
cosmological constant, we have computed the dimension of the Hilbert space Hrel

non-pert relevant
for the description of an observer’s experience in a closed universe and in a two-sided black
hole, and found it is much larger than the corresponding global Hilbert spaces Hnon-pert
computed with the old rules for the gravitational path integral. We then studied the properties
of this Hilbert space, including its factorisation, the positivity of the inner product defined
by the path integral with our new rules, and the presence of null states.

We also studied various relational observables probing the experience of the observer. In
the closed universe setting, we computed correlation functions between points on the observer’s
worldline. In the two-sided black hole setup, we studied the length of the Einstein-Rosen
bridge and the center-of-mass collision energy between an observer and a shockwave behind
the horizon. The behavior of these observables (except the length of the Einstein-Rosen
bridge) is substantially modified in our new framework with respect to the global picture for
the gravitational path integral in the absence of an observer: non-perturbative corrections
are typically smaller from the point of view of the observer than in the global perspective.
Nevertheless, such non-perturbative effects can become important at leading order for the
observer, giving in-principle testable corrections to their experience, when some scale in the
setup scales exponentially with S0. Such corrections can be critical even when the proper time
that the observer travels in the spacetime is O(1). For example, in the case of an observer
falling into a two-sided black hole, the observer travels an O(1) proper time until they cross
the horizon. Once they cross the horizon of a an old black hole, they could see (with tragic
consequences) that both the length of the Einstein-Rosen bridge and the center-of-mass
collision energy with a shockwave sent in from the other side receive large non-perturbative
corrections when the age of the black hole scales as eS0 . It would be interesting to see if we
also encounter large non-perturbative corrections to the two-point function measured at O(1)
proper times along the observer’s worldline in the closed universe. In this case, contributions
from arbitrarily long winding geodesics become important close to the singularity leading to
an accumulation of divergences; whether this accumulation of divergences can be resolved
by non-perturbative corrections remains to be seen.

The results of this paper open up several new avenues of research. A first important
task is to generalize our results beyond the two-dimensional toy-model discussed here to
higher-dimensional theories of gravity. We remark that, although they also immediately
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hold for pure JT gravity, all our results were obtained in JT gravity with matter. In this
context, most of the wormhole geometries considered in this paper, e.g., in all our resolvent
calculations, are saddles of the gravitational path integral [84, 110]. Similar calculations that
do not rely on off-shell contributions to the gravitational path integral can also be carried
out in higher dimensions, see, e.g., [26, 27, 75, 111, 112]. We, therefore, expect the extension
of our results to these setups to be rather straightforward.

In the rest of this section, we will explore additional future directions. Specifically,
in section 7.1, we discuss the relationship between our proposal and other approaches to
relational dynamics in quantum gravity and draw an analogy between the quantization of
gravity in the presence of an observer and Chern-Simons theory in the presence of sources.
In section 7.2, we comment on the consequences of our results for the holographic description
of the experience of a gravitating observer. Finally, in section 7.3, we explain how to extend
our results to describe the experience of an observer in de Sitter space.

7.1 Relational dynamics and the gravitational path integral

An interesting future direction is to study the relationship between our proposal and other
formalisms for describing relational dynamics in gravitating systems. As it was recently
discussed in detail [101], physical states in quantum gravity can be represented in two
different ways. The first one is in terms of co-invariants, i.e., equivalence classes of states
under the action of the gravitational constraint. In this approach, relational dynamics emerges
naturally as gauge evolution within a given equivalence class [101]. This is the approach used
in [56]. The second one is to define physical states to be annihilated by the gravitational
constraint operators [100, 113, 114]. These states are sometimes called “invariants”. In
this case, relational dynamics can be studied by selecting a suitable subsystem to play the
role of a clock (i.e., an observer) and describing physics with respect to this clock using
the Page-Wootters formalism. [73, 115, 116].51 At least at the perturbative level, the two
approaches describe the same physics

We expect that our gravitational path integral approach to be compatible with these
relational approaches at the perturbative level, and, in particular, it implements the co-
invariant approach, which arises naturally when defining states in terms of boundary conditions
on geodesic boundaries [101]. On the other hand, our prescription is also well-defined non-
perturbatively and should therefore represent a non-perturbative extension of these ideas.
We leave a more precise characterization of the role of our proposal in the description of
relational dynamics in quantum gravity to future work.

Before moving on to discuss implications for holography, we would like to point out an
analogy between our proposal for the gravitational path integral from the point of view of an
observer and Chern-Simons theory in the presence of a source.52 Exact quantization in the
presence of a detector is an old and well-studied problem in quantum field theory. In the
course of this work, we found it useful to draw analogies to models where this quantization

51We thank Elliott Gesteau and Ronak Soni for emphasizing this point to us.
52A similar comparison between Chern-Simons and the quantum gravity of closed universes was made

in [117, 118].
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can be accomplished exactly. One such case is Chern-Simons (CS) theory in the presence of
sources. CS is a topological 3D gauge theory of a Lie algebra-valued connection [119, 120].53

Pure JT gravity and pure CS are both theories with constraints. In JT, the most
commonly remarked upon constraint is H0, defined in equation (2.5), which involves the left
and right boundary Hamiltonians in a two-sided black hole in the absence of matter. In CS,
the constraint dictates that the field strength vanishes, or, equivalently, that the connection
is flat. We have two options when attempting to implement these constraints [119]. We could
“quantize then constrain” (also known as Dirac quantization [100]) by quantizing the phase
space of field configurations before implementing the constraint as an operator whose kernel
determines physical states. Alternatively, we could “constrain then quantize” by restricting to
the subspace of configurations satisfying the constraint before quantization. When we “con-
strain then quantize”, the constraint is a manifestly vanishing operator on physical states, and
it is natural to refer to this as the Hilbert space of invariants, as described above. The states
in the kernel of the constraint in the “quantize then constrain” approach are, by definition,
invariants. However, this approach is most rigorously defined with respect to co-invariants
to account for cases where the kernel of the constraint contains non-normalizable states.54

The addition of matter modifies the constraint. That modification is determined by
how the underlying symmetry acts on the coupled matter. This is a gauge symmetry for a
generic quantum field theory, and the background isometry in the specific case of gravity.
We saw part of how this modification manifests gravitationally in equation (2.19). In CS,
the modification is the addition of a source current density. Regardless of our quantization
procedure, the Hilbert space in the presence of matter will be different because the definition
of a state has changed. However, simply adding matter is not enough to make observations.
Observables in gravity need to be dressed to a clock. Similarly, observables in CS are Wilson
lines, holonomies of the gauge connection traced in a particular representation. Just as gravity
need not provide us a clock, a priori CS does not dictate a representation [122]. A “detector”
is a special type of matter field that is localized to a worldline Γ and tells us how to calculate
observables. In gravity, that detector is the observer, and in CS, it is the source charge.

The similarities between these formalisms are abundant. CS assigns the source a Hilbert
space Hobs that lives on their worldline [123, 124]. The field configuration space is manifestly
the direct product Hobs ×Hrel

non-pert where Hrel
non-pert is the space of allowed gauge connections.

Observables are calculated via a path integral with Γ acting as an additional boundary. Our
new rules are justified by this order of operations. Choosing a location for the detector before
path integration dictates that this degree of freedom is not subject to the usual dynamics
of the theory. A source so-defined is not influenced by external fields, just as the observer
worldline must connect bra and ket independent of topology change. As we have seen, these
rules mean that the Hilbert space can change in the presence of a detector. A once trivial
theory unveils hidden dynamics in the presence of an observer. We give additional details
of this analogy in appendix D.

53We provide a more complete review of CS in appendix D and summarize some of the motivating similarities
here.

54It is not generally known whether these procedures result in identical Hilbert spaces [100, 121], but these
toy models are simple enough that we will neglect this concern. Specifically, in the case of JT, one can quantize,
constrain, and define invariants at the cost of division by the infinite volume of the gauge group [96].
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Figure 16. Examples of two-dimensional boundary configurations relevant for studying dressed
observables in a closed universe (left figures) or in a two-sided black hole (right figures). The
undeformed CFT is placed on all tori (asymptotic boundaries); a future task is to find the precise
deformation of the CFT to be placed on the red cylinders (boundaries of the observer worldvolumes).
The first figure in each set assumes that the worldvolume of each observer is bounded by the thin red
cylinder, while the second figure in each set assumes that the observer is circularly symmetric and
their worldvolume is bounded by the two red cylinders. The latter case is related through dimensional
reduction to the analysis performed in this paper.

7.2 Lessons for holography

One particularly interesting future direction is understanding the holographic dual theory
that arises from our proposal and describes the experience of the observer. In AdS/CFT

— our best-understood example of holography — the dual theory lives on the asymptotic
AdS boundary. For instance, in the two-sided black hole case, it is given by two entangled
CFTs living on the two asymptotic boundaries [125]. Despite its many successes, this class of
setups presents some limitations. Most notably, it is unclear how to holographically describe
the experience of a bulk observer in generic settings [54]. This is particularly true when the
dynamics experienced by a bulk observer are not directly related to the dynamics of the
boundary CFT. Paradigmatic examples of this fact are bulk observers in the interior of a black
hole at late times or moving within a single Wheeler-DeWitt patch of a pure AdS spacetime.
In both cases, the experience of the observer is not uniquely determined from the holographic
dual theory. In the black hole case, this is a consequence of the non-isometricity of the
bulk-to-boundary map [86, 87]. The most extreme example of these ambiguities is provided by
an isolated closed universe, in which there is no boundary where to define a dual theory at all.

Our proposed modification of the gravitational path integral in the presence of an
observer suggests a path to address this issue. As we have discussed throughout this paper,
the worldline of the observer is treated as an additional timelike boundary in the gravitational
path integral and thus provides a natural location for the holographic dual theory. In less
idealized settings, the worldline should be replaced by a codimension-0 worldvolume for the
observer, which defines a codimension-1 timelike boundary in the spacetime where the dual
theory would be defined, see figure 16. The results of section 4 about the dimension and
factorisation of the quantum gravity relational Hilbert space Hrel

non-pert (see also appendix C)
are compatible with this intuition.

In the closed universe case, dim (Hnon-pert) = 1 in the absence of an observer, which can
be interpreted as the absence of a dual theory (whose Hilbert space must be isomorphic to the
non-perturbative quantum gravity Hilbert space). On the other hand, dim

(
Hrel

non-pert

)
= d2

when we fix the worldline (or, more generally, the worldvolume) of the observer. The fact
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that Hrel
non-pert in the presence of matter factorises into two Hilbert spaces of dimension d

to the left and right of the observer (see appendix C.1 for details) signals that the dual
description could consist of a pair of non-interacting holographic theories living on the left
and right boundaries of the observer’s worldvolume (which in the two-dimensional case under
examination would simply be a thin strip). Similarly, in the two-sided black hole case in
the presence of matter, dim (Hnon-pert) = d2 without an observer and dim

(
Hrel

non-pert

)
= d4

when fixing the worldline of the observer. Hrel
non-pert now factorizes into a tensor product of

four Hilbert spaces (see appendix C.2). This is compatible with having two additional dual
theories on the boundaries of the observer’s worldvolume besides those living on the two
asymptotic AdS boundaries. A generic two-sided black hole state, in this case, would be
dual to an entangled state of four CFTs with a specific four-partite entanglement structure
determined by the operator insertions associated with the observer and matter.

What could this holographic theory look like? One important observation is that the
worldline of the observer, or, more accurately, the boundary of their worldvolume, should not
be regarded as an asymptotic boundary; rather, it is a timelike boundary embedded into the
bulk spacetime. Therefore, it seems plausible that the holographic theory living on such a
boundary is not an ordinary CFT but some deformed theory, perhaps similar to TT -deformed
CFTs [60, 126–129] relevant for the holographic description of spacetimes in the presence of
timelike boundaries. It would be interesting to further explore this possibility.

As we have discussed in this paper, the Hilbert space Hrel
non-pert computed by the modified

gravitational path integral is the Hilbert space relevant for the description of relational
dynamics with respect to the observer. In other words, it is the Hilbert space needed to
capture the observer’s experience in the bulk. The Hilbert space of the holographic theory
living on the boundary of the observer’s worldvolume (plus those on any asymptotic boundary)
would clearly be isomorphic to Hrel

non-pert. This implies that, unlike ordinary AdS/CFT, the
experience of the bulk observer would certainly be encoded in such a dual theory. This
would, therefore, be a consistent step forward in the description of local bulk physics in
holography. Notice that this holographic approach could also help us extend our results
beyond the toy model of this paper to higher dimensional settings in which the gravitational
path integral is not as well understood.

7.3 Observers in de-Sitter space

Our results for the gravitational path integral in the presence of an observer can be extended to
de Sitter JT gravity. Unlike the AdS-JT case discussed in this paper, there are no asymptotic
boundaries in Euclidean signature in dS-JT gravity. Nonetheless, a generic state55 |a,K,∆(i)

O ⟩
can be specified in terms of the length a and extrinsic curvature K of an initial slice of
Euclidean dS2 where we insert the operator O(i)

O of scaling dimension ∆(i)
O associated with

the observer. The resulting state — which is prepared on the reflection-symmetric slice of the
Euclidean geometry computing the norm of the state ⟨a,K,∆(i)

O |a,K,∆(i)
O ⟩ — can then be

evolved in Lorentzian time, yielding two-dimensional Lorentzian de Sitter, see figure 17. We
remark that this set of states |a,K,∆(i)

O ⟩ includes (but is not limited to) the Hartle-Hawking
55In this discussion, we will consider the pure JT gravity case for simplicity, but the inclusion of matter

does not alter our conclusions.
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Figure 17. The Euclidean preparation (bottom half) and subsequent Lorentzian evolution (top half)
of a de Sitter state |a,K,∆(i)

O ⟩ specified by the length a and extrinsic curvature K of an initial slice
at Euclidean time τ = τi where the observer is inserted. The Lorentzian part of the evolution from
the Euclidean sphere’s equator at τ = 0 (depicted in blue) yields Lorentzian dS2, with a spacelike
asymptotic boundary at Lorentzian time t → ∞. Our set of states |a,K,∆(i)

O ⟩ includes (but is not
limited to) the smooth Hartle-Hawking no-boundary state.

no-boundary state [7, 130].56 In fact, for generic boundary conditions on a given time slice,
the Euclidean time evolution to the past of that slice does not yield a smooth no-boundary
geometry but rather a punctured sphere.

The inner product between two states can be computed using our rules for the gravitational
path integral in the presence of an observer (see figure 18(a)). Similarly, we can compute
higher moments of an overlap. With our rules, the leading order correction to the product of
two overlaps is given by the connected geometry depicted on the right of figure 18(b), which is
a sphere with four holes. This geometry computes the variance of the overlap, which is then

|⟨a′,K ′,∆(j)
O |a,K,∆(i)

O ⟩|2 −
∣∣∣∣⟨a′,K ′,∆(j)

O |a,K,∆(i)
O ⟩
∣∣∣∣2 = δijO(e−2S0). (7.1)

Following the discussion at the beginning of section 2.2, this suggests a dimension of the
quantum gravity relational Hilbert space

dim
(
Hrel

non-pert

)
= O(e2S0) (7.2)

for global de Sitter. Similar to the closed universe in AdS-JT discussed at the beginning
of section 3, this result should be contrasted with the O(1) variance and one-dimensional
Hilbert space we would obtain with the old rules by allowing the observer’s worldline to
connect between all bras and kets in the gravitational path integral.

It would be interesting to explore these results in more detail, determine the precise
dimension of the Hilbert space Hrel

non-pert in dS-JT gravity, and study relational observables in
de Sitter using our proposal. In fact, a prescription similar to our proposal for how to treat

56The Hartle-Hawking no-boundary state is obtained through the fact that on slices of constant K, K
determines a on S2 with

a = 2π√
1 +K2

,

for spheres with R = 2. States that do not satisfy this relation between K and a are not defined on a smooth
S2 and are therefore different from the no-boundary state. An analogous property holds in AdS2 where on
surfaces that have the topology of a disk, K also determines the proper length of the curve [131].
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Figure 18. The gravitational path integral in the presence of an observer for de Sitter spacetime. A
state is defined in terms of the length a and extrinsic curvature K of an initial slice where we insert
the observer with scaling dimension ∆O. The worldline of the observer (depicted in red) must connect
a bra and the corresponding ket when computing moments of an overlap. (a) The overlap ⟨a′,K ′|a,K⟩
between two states. (b) The square of an overlap |⟨a′,K ′|a,K⟩|2 in the presence of an observer. The
variance of the overlap is given by the connected geometry on the right, namely a sphere with four
holes, and is therefore O(e−2S0). This suggests a Hilbert space dimension dim

(
Hrel

non-pert
)
= O(e2S0).

We plan to explicitly compute this dimension in future work.

an observer was discussed in the context of dS-JT gravity in [40]. There, it was shown that
treating the observer as a non-perturbatively well-defined boundary condition in the path
integral resolved apparent contradictions between the GPI and the no-cloning theorem. The
generalization to higher dimensional setups is also of great interest and could set the stage for
a non-perturbative generalization of the results obtained in [56]. A holographic realization
of this setup similar to that suggested in section 7.2 could represent a new framework for
de Sitter holography.

Finally, our results do not depend on specific global properties of the spacetime; instead,
they are centered on the experience of a gravitating observer. Therefore, they could be
generalized to describe quantum gravity in generic settings, including realistic cosmological
spacetimes. We leave the investigation of these intriguing new avenues to future work.
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A Resolvents and replicas

In this appendix we derive the analytic properties of the resolvent used in the main text.
Along the way, we also give a slightly different derivation of the Hilbert space dimension
starting from the Schwinger-Dyson equation for the resolvent. We start by returning to the
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toy model which gave equation (2.35) and considering the maximally mixed state on H,57

ρ ≡
K∑

i=1
|vi⟩ ⟨vi| . (A.1)

We suspect that ρ is not full rank due to wormhole corrections and seek to calculate

dim(H) = rank(ρ) (A.2)

by using replicas

dim(H) = lim
n→0

TrHρn. (A.3)

The trace is computed using the non-perturbative inner product and we assume TrH ≈
TrHnon-pert .58

We emphasize some technical details before proceeding to the calculation. Null states
are introduced into H by taking S0 finite (cf. section 5). We see that the replica limit does
not commute with the choice to send S0 → ∞ by considering

0 = lim
n→0+

⟨λ|λ⟩n ̸= lim
n→0+

⟨λ|λ⟩n = 1 (A.4)

for a null state |λ⟩. The first equality is essential to counting the dimension of the non-
perturbative Hilbert space. Otherwise, we would always find a space of dimension K. With
this operational understanding, equation (A.3) counts the number of non-zero eigenvalues of ρ.

To perform this calculation, we will need to calculate arbitrary powers of the Gram matrix

Mij ≡ ⟨vi|vj⟩ (A.5)

which is just the metric on H. The rank of the Gram matrix is the same as that of ρ.
The negative powers of the Gram matrix are not well defined since the matrix is singular.

We introduce the pseudo-inverse to remedy this. For an operator A acting on H the
Moore-Penrose pseudo-inverse A−1 is defined such that

AA−1A = A (A.6)

and (A−1)−1 = A. Although unnecessary for our purposes, it can be shown that A−1 is
unique in the space of observables. Furthermore, we have

Claim. TrHA−1A = TrHAA−1 = rank(A)

Proof. Let I = A−1A. By construction, A and A−1 share a kernel so I is of the same rank
as A. Moreover, this operator is a projection

I2 = A−1AA−1A = A−1A = I (A.7)
57We temporarily make use of boldface for operators to distinguish them from their traces.
58The equality is approximate due to coarse-graining. Taking TrHnon-pert requires specifying a UV theory.

Instead, we calculate TrH which calculates an average over an ensemble of theories [11, 13, 25].
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so it admits a rank factorization into some I = LR where L is left invertible and R is right
invertible. Because I is a projection, RL must be the identity matrix of dimension rank(I).
By cyclicity of the trace

TrHI = rank(I). (A.8)

The argument follows similarly for I = AA−1.

As a corollary we have that M−1M ̸= ρ since

rank(M) = TrHM−1M ̸= TrHρ = K (A.9)

where the third equality holds assuming normalized {|vi⟩}. This clarifies that ρ is never a
resolution of the identity if we endow H with the non-perturbative inner product.

The correct limit of the Gram matrix is

dim(H) = lim
n→0

TrHρn = lim
n→−1

TrHMnM . (A.10)

We will compute this limit using the resolvent of the Gram matrix

Rij(λ) ≡
( 1
λI− M

)
ij
,

= 1
λ

(
δij +

1
λ
(M)ij +

1
λ2

(M2)ij + · · ·
) (A.11)

The power series is taken literally when |λ| ≫ ||M || and the analytic continuation is assumed
outside of the radius of convergence.

Given a complex function f(λ) that is analytic in the interior of some contour, we
can define

f(A) =
∮

dλ

2πi
f(λ)
λI− A

(A.12)

to be its generalization to square matrices. For holomorphic f , this definition is independent
of the choice of contour and matches the standard matrix function. The pseudo-inverse is
not analytic on general operators so we cannot use equation (A.12) to calculate it. Instead,
we consider functions of the form

f(A)M =
∮

dλ

2πi
f(λ)M
λI− A

(A.13)

which are analytic on operators A with ker(A) = ker(M). The contour is irrelevant for
holomorphic f(λ). Conversely, we can extend to non-holomorphic f by a choice of contour.
The contour which correctly assigns equation (A.4) for f(λ) = limn→−1 λ

n ·λ is C = C∞ ⊔C0
(cf. figure 3). Equation (A.10) is of this form so we aim to calculate

dim(H) = Tr
[∮

C

dλ

2πiλ Rij(λ)Mji

]
= Tr

[∮
C

dλ

2πi Rij(λ)
]

(A.14)

where repeated indices are summed over. The second equality follows since f(λ) is holomorphic
in the interior of C.
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The integrand can be rewritten as

(RM)ij = 1
λ
(M)ij +

1
λ2

(M2)ij + · · · , (A.15)

= λRij − δij . (A.16)

In appendix 2 and section 4, we find that the trace of the right-hand-side can be rewritten
using a SDE of the form

λR = K +
∫
µ(E⃗) y(E⃗)R

1− y(E⃗)R
(A.17)

where E⃗ and µ(E⃗) generalize the energy bases and measures introduced in sections 2 and 4.
We also generalize by defining

D =
∫
µ(E⃗). (A.18)

Several useful properties follow. Proofs are given at a physicist’s level of rigor.

Claim. The resolvent is finite on C/0.

Proof. It suffices to show that λR(λ) < ∞ on C. Suppose otherwise. Then there is some
nonzero λ such that yR = 1 meaning y vanishes. This can only happen if γ∆ vanishes but
this is impossible by the properties of the Γ function (cf. equation (2.24)).

As a corollary we have that the function fy(λ) = yR
1−yR has no poles for y ∈ R+.

Claim. The resolvent has the following structure as λ→ 0

R(λ) ∼

−R0(K) if K ≤ D
K−D

λ , otherwise
(A.19)

where R0(K) is a finite positive function on 0 ≤ K ≤ D.

Proof. By definition, if R is finite at λ = 0 then it is real and non-positive. Suppose that
−∞ < R(0) < 0 and let R0 = −R(0). The SDE becomes∫

µ(E⃗) yR0
1 + yR0

= K. (A.20)

Since yR0 > 0, the integrand is less than one and this ansatz can only work for K ≤ D. In
this domain we take this as a definition for R0(K). Now suppose that we encountered a
singularity so that

lim
λ→0

R ∼ R0,n

λn
(A.21)

with R0,n ̸= 0. By the SDE

R0,n ∼ λn−1
(
K +

∫
µ(E⃗) yR0,n

λn − yR0,n

)
(A.22)
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so at most R has a simple pole at λ = 0 with residue

R0,n =

K −D if n = 1,
0 otherwise.

(A.23)

As a corollary we have that

fy(0) =


−yR0(K)
1+yR0(K) if K ≤ D,

−1 otherwise.
(A.24)

For completeness, we also verify

Claim. The resolvent has no branch points for λ ∈ {0,∞}.

Proof. Differentiating the SDE gives

R(λ) = dR

dλ

(∫
µ(E) y

(1− yR(λ))2 − λ

)
. (A.25)

At a branch point, we must have

λ =
∫
µ(E) y

(1− yR(λ))2 . (A.26)

For λ = 0 this requires y to vanish which is ruled out by equation (2.24). As λ → ∞ this
requires yR = 1. This is ruled out by the first claim.

As a corollary we have that fy has no branch points for λ ∈ {0,∞}. We will assume without
proof that fy has no branch cuts in a neighborhood of these points. This is not always true
(e.g., a closed universe without observers) and should be checked case-by-case.

Plugging the trace of (A.15) into equation (A.14) using equation (A.17) gives

dim(H) =
∫
µ(E⃗)

∮
C

dz

2πiλ fy(λ) (A.27)

where C = C∞ ⊔ C0 is a contour defined in a neighborhood without branch points. We
pick up no contribution from the C∞ integral since the integrand goes as 1

λR ∼ 1
λ2 for

large λ. The residue at λ = 0 is −fy(0) since C0 wraps clockwise. At last, performing
the phase space integral gives

dim(H) =

K if K ≤ D,

D otherwise
(A.28)

which confirms the results of the main text.
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B The Hilbert space of two-sided black holes

We now move on to studying the non-perturbative Hilbert space of two-sided black holes.
We work in the limit K → ∞, e2S0 → ∞ with K/e2S0 = O(1). We study spaces spanned
by states carrying an unspecified matter index i, a fixed scaling dimension ∆, and a fixed
asymptotic boundary length βL = βR = β/4 to the left and right of the matter insertion

Hnon-pert(K) = Span {|qi⟩ ; i ∈ {1, · · · ,K}} . (B.1)

As discussed in the main text, these conventions are established purely for notational
convenience.59

Inner products are calculated using the topological expansion

⟨qi|qj⟩ = = δij


+ + · · ·


(B.2)

Note how the asympotic boundaries are forced to connect while the matter insertions float
freely until the geometry is filled in with the gravitational path integral. The second moment
is calculated similarly

| ⟨qi|qj⟩ |2 =

= δij


+O(e−2S0)



+ e−2S0


+O(e−2S0)


.

(B.3)

The pinwheel (2.38) is the generalization to the n-th moment

⟨qi1 |q12⟩ · · · ⟨qin |qi1⟩ = Zn =
∫
dsLdsRρ0(sL)ρ0(sR) yn

∆(sL, sR) (B.4)

59For example, one could equivalently define

Hnon-pert(K) = Span {|qi⟩ = |∆i;βL = βR = β/4⟩ ; i ∈ {1, · · · ,K} and ∆i ≈ ∆}

for fixed ∆ and β. Basis independence is discussed in appendix B of [74].

– 75 –



J
H
E
P
0
5
(
2
0
2
5
)
0
5
9

where
y∆(sL, sR) = e−S0e−

βs2
L

4 e−
βs2

R
4 γ∆(EL, ER). (B.5)

We are free to drop indices and lengths when defining the pinwheel thanks to our choice
of states {|qi⟩}.

Already, we can see why the Hilbert space dimension is reduced by the non-perturbative
inner product. The first moment is proportional to δij while higher moments are nonzero
even when i ̸= j. These extra terms correspond exclusively to wormhole corrections. We
ignored them in section 2.1 because they are non-perturbatively suppressed by factors of e−S0 .
Undoing that choice is precisely what gives us a finite-dimensional Hilbert space. We introduce

d ≡ eS0

∫
dEρ0(E) (B.6)

as the relevant parameter for discussions of the Hilbert space dimension, where E = s2/2 and
the relationship between ρ0(E) and ρ0(s) is given in equation (2.10). For this parameter to be
finite we need to work in an arbitrary but finite energy window E ∈ (Emin, Emax). To leading
order in eS0 , the variance is given by the first connected wormhole geometry in equation (B.3)

σ2 = | ⟨q|qj⟩ |2 −
∣∣∣⟨qi|qj⟩

∣∣∣2 = O(e−2S0). (B.7)

Using equation (3.7) gives us an estimate dim(Hnon-pert) = O(d2). This result is in agreement
with our semiclassical understanding of this system as a two-sided black hole where each
horizon carries an entropy S0.60

We once again refer to a resolvent for a more detailed analysis. The n-th power of the Gram
Matrix (Mn)ij is given by pinwheel boundary conditions where all but two adjacent indices are
identified and summed over. This means that we can write the resolvent diagrammatically as

= + + + · · ·

= + +



+

+



+ · · ·

(B.8)
60In non-perturbative pure JT gravity, the constraint H0 (2.5) reduces the dimension of the Hilbert space

by imposing that the left and right horizons are highly entangled. This gives dim(Hnon-pert) = O(eS0) [38].
We saw in equation (2.19) that the inclusion of matter breaks the constraint, allowing us to explore the full
Hilbert space of the two-sided black hole.
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We can reorganize this sum recursively based on how many boundaries the first boundary
connects to. This yields the following Schwinger-Dyson equation (SDE)

= +

+ + · · ·
(B.9)

For a fixed topology, we are ignoring terms like

(B.10)

because they are subleading in K compared to a cyclic contractions of the indices. This
means that internal factors of the resolvent are traced over.

The diagrams translate to the following equations

λRij(λ) = δij +
∞∑

n=1
ZnR

n−1(λ)Rij(λ),

= δij + e2S0
∑∫

dsLdsRρ(sL)ρ(sR) yn
∆(sL, sR)Rn−1(λ)Rij(λ).

(B.11)

Tracing over the external indices gives

λR = K + e2S0
∑∫

dsLdsRρ(sL)ρ(sR) yn
∆(sL, sR)Rn(λ),

= K + e2S0

∫
dsLdsRρ(sL)ρ(sR)

y∆R(sL, sR)
1− y∆(sL, sR)R(λ)

.
(B.12)

This SDE is of the form described in equation (A.17). By the results of appendix A, we obtain61

dim(Hnon-pert(K)) =

K if K ≤ d2,

d2 otherwise.
(B.13)

For K < d2, the {|qi⟩} states span a K-dimensional subspace of Hnon-pert. When K > d2, the
states become overcomplete and the subspace dimension saturates at dim(Hnon-pert(K)) = d2.
Since this result is independent of basis, we conclude that dim(Hnon-pert) = d2. The difference
between the number of states and the dimension of the span is K − d2, the residue of the
resolvent at λ = 0. Equivalently, the Gram matrix M has eigenvalue λ = 0 with multiplicity
K − d2. We call a state in ker(M) a null state [16, 38]. A detailed description of these
states is provided in section 5.

61We could also compute equation (2.42) using the integration contour given in figure 3. This calculation is
very similar to that explicitly carried out in section 4.1, to which we refer for details.

– 77 –



J
H
E
P
0
5
(
2
0
2
5
)
0
5
9

C Factorisation of the Hilbert space in the presence of an observer

In this appendix, we will show that the non-perturbative quantum gravity relational Hilbert
space Hrel

non-pert factorises as discussed at the end of sections 4.1 and 4.2.

C.1 Closed universe

Given the resolvent analysis carried out in section 4.1, we can now show that the non-
perturbative, relational Hilbert space Hrel

non-pert for JT gravity coupled to matter in a closed
universe factorises:

Hrel
non-pert = Hrel

non-pert,l ⊗Hrel
non-pert,r. (C.1)

Here Hrel
non-pert,l and Hrel

non-pert,r denote the Hilbert spaces to the left and right of the observer.
To show this, let us follow [74] and show that62

trHrel
non-pert

(klkr) = trHrel
non-pert,l

(kl) trHrel
non-pert,r

(kr), (C.2)

where kl and kr are operator insertions to the left and right of the observer. In particular, we
will consider insertions of kl and kr on an asymptotic boundary, and focus on the simple case
in which kl = e−βlHl and kr = e−βrHr , see figure 19, where Hl and Hr are the generators of
translations along the asymptotic boundary on the left and right of the observer. Our results
can be generalized to arbitrary operators kl, kr, but this requires dressing the operators
to the observer’s worldline, as we discussed in section 6.63 If we start with one of the
states |ψi⟩, i = 1, . . . ,K considered above — for which the boundary length is fixed to
be β — the boundary associated with the resulting state |ψi,β̃⟩ = klkr |ψi⟩ will then have
length β̃ = β + βl + βr.

The trace over the non-perturbative, relational Hilbert space spanned by K matter basis
states Hrel

non-pert(K) is given by [74]

trHrel
non-pert(K)(klkr) = lim

n→−1

∑
ij

(Mn)ij ⟨ψj |klkr|ψi⟩, (C.3)

where Mij is again the Gram matrix of overlaps and M−1 is its generalized inverse. To relate
the trace to the resolvent, we can contract both sides of equation (2.40) with ⟨ψj |klkr|ψk⟩
and obtain

∑
j

Rij(λ)⟨ψj |klkr|ψk⟩ =
1
λ

∞∑
n=0

∑
j (Mn)ij ⟨ψj |klkr|ψk⟩

λn
. (C.4)

62Technically, we will show this relationship using the gravitational path integral, and therefore in terms of
averages over the dual random matrix ensemble.

63In general, when considering a correlation function ⟨ψi|klkr|ψj⟩, we need to specify where the operators
are acting with respect to the time read by a clock along the worldline. For instance, we must specify whether
they are acting on the boundary associated with the bra or the ket. We will clarify this procedure in section 6.
The operators e−βH we consider here do not require dressing for our purposes because changing the length of
an asymptotic boundary in a bra or the corresponding ket yields the same result for the overlap between the
two states and its moments, which is all we will need. This is manifest from equation (C.7), which only depends
on the sum of the lengths of the bra and ket asymptotic boundaries to the left and right of the observer.

– 78 –



J
H
E
P
0
5
(
2
0
2
5
)
0
5
9

Figure 19. Boundary conditions for a closed universe state prepared by the insertion of the observer,
a matter operator of flavor i, and operators kl = e−βlHl and kr = e−βrHr to the left and right of the
observer. The insertion of kl and kr in a state with boundary length β/2 to the left and right of the
observer (left picture) is equivalent to a state with boundary length β/2+βl to the left of the observer
and β/2 + βr to the right of the observer (right picture).

Figure 20. Genus-zero pinwheel geometry contributing to the n = 2 term ⟨ψl|ψi⟩⟨ψi|ψj⟩⟨ψj |klkr|ψl⟩
on the right hand side of equation (C.4).

The trace can then be obtained by the residue integral

trHrel
non-pert(K)(klkr) = lim

n→−1

1
2πi

∮
C
dλλn

∑
ij

Rij(λ)⟨ψj |klkr|ψi⟩. (C.5)

The integral here is on the same contour C = C0 ∪ C∞ depicted in figure 3.64 The integrand
in equation (C.5) can be obtained by a diagrammatic expansion of equation (C.4). This is
very similar to the one used above for the resolvent. The main difference is that geometries
contributing the n-th term in the sum have 2n+ 2 boundaries, with 2n+ 1 boundaries of
length β and one boundary of length β̃. The leading connected contribution is given by a
genus-zero pinwheel with an observer insertion and a matter insertion on each of the 2n+ 2
boundaries, depicted in figure 20. This geometry gives a contribution65

Zclosed
n+1 (kl, kr) = e2S0

∫
dsldsrρ0(sl)ρ0(sr)x̃n(sl, sr)x̃k(sl, sr) (C.6)

64Also in this case, the contour must exclude the origin because we must exclude any vanishing eigenvalues
when defining the generalized inverse.

65Here we label the energies by l and r to indicate the patches to the left and right of the observer. These
are the same patches that we labeled by 1 and 2 in the calculation of the Hilbert space dimension in section 4.1,
see the caption of figure 7.
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where x̃ is given in equation (4.2) and x̃k is defined as

x̃k(sl, sr) = e−2S0e−
(β+βl)s2

l
2 e−

(β+βr)s2r
2 γ∆O

(sl, sr)γ∆m(sl, sr). (C.7)

After setting i = k and summing over i, the Schwinger-Dyson equation obtained from the
diagrammatic expansion of equation (C.4) reads

∑
ij

Rij(λ)⟨ψj |klkr|ψi⟩ =
∞∑

n=0
Zclosed

n+1 (kl, kr)Rn+1(λ)

= e2S0

∫
dsldsrρ0(sl)ρ0(sr)

R(λ)x̃k(sl, sr)
1−R(λ)x̃(sl, sr)

.

(C.8)

We can now finally compute trHrel
non-pert(K)(klkr) using equation (C.5):

trHrel
non-pert(K)(klkr) =

e2S0

2πi

∫
dsldsrρ0(sl)ρ0(sr)x̃k(sl, sr)

∮
C

dλ

λ

R(λ)
1−R(λ)x̃(sl, sr)

. (C.9)

Because R(λ) ∼ K/λ2 for λ → ∞, the integral over the counterclockwise contour C∞ at
infinity vanishes, and we can focus solely on the integral over the clockwise contour C0 around
λ = 0. As we have discussed above, if we consider K < d2 basis states, R(λ) has no poles.
We can thus write R(0) = −R0(K) [74] and obtain

trHrel
non-pert(K)(klkr) = e2S0

∫
dsldsrρ0(sl)ρ0(sr)

R0(K)x̃k(sl, sr)
1 +R0(K)x̃(sl, sr)

K < d2. (C.10)

In this case, the trace clearly does not factorise due to the non-trivial dependence of γ∆O
(sl, sr)

and γ∆m(sl, sr) on sl and sr, see equation (2.24). The reason for this lack of factorisation is
that K < d2 states do not span the full quantum gravity relational Hilbert space Hrel

non-pert,
but rather an arbitrary subspace of Hrel

non-pert, which need not factorise in general.
On the other hand, for K > d2, Hrel

non-pert(K) = Hrel
non-pert, namely, the K states span the

entire quantum gravity relational Hilbert space. Note that for K > d2, R(λ) has a pole at
λ = 0 and therefore drops out of the integral over C0. We then obtain

trHrel
non-pert(K)(klkr) = trHrel

non-pert
(klkr) = e2S0

∫
dsldsrρ0(sl)ρ0(sr)

x̃k(sl, sr)
x̃(sl, sr)

=
(
eS0

∫
dslρ0(sl)e−

βls2
l

2

)(
eS0

∫
dsrρ0(sr)e−

βrs2r
2

)

= trHrel
non-pert,l

(kl)trHrel
non-pert,r

(kr) K > d2

(C.11)

We then conclude that the full quantum gravity relational Hilbert space Hrel
non-pert factorises

into a Hilbert space to the right of the observer and a Hilbert space to the left of the observer.

C.2 Two-sided black hole

Similarly, it is simple to argue that the Hilbert space Hrel
non-pert of two-sided black holes

factorises into a tensor product of four Hilbert spaces

Hrel
non-pert = Hrel

non-pert,R ⊗Hrel
non-pert,r ⊗Hrel

non-pert,L ⊗Hrel
non-pert,l, (C.12)
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Figure 21. Boundary conditions for a two-sided black hole state prepared by the insertion of the
observer, two matter operators to the left and right of the observer, and operators kl = e−βlHl ,
kr = e−βrHr , kL = e−βLHL , kR = e−βRHR . The insertion of kl, kr, kL, kR in a state with every
boundary segment of length β/8 (left picture) is equivalent to a state with boundary segments of
length β/8 + βl, β/8 + βr, β/8 + βL, and β/8 + βR (right picture).

where Hrel
non-pert,R, Hrel

non-pert,L are associated with the right and left asymptotic boundaries,
and Hrel

non-pert,r, Hrel
non-pert,l, with the right and left sides of the observer. Here we will only

sketch the main steps of the argument, because it is very similar to that used to show the
factorisation of Hrel

non-pert in the closed universe case.
We can consider the insertion of four operators kl = e−βlHl , kr = e−βrHr , kL = e−βLHL ,

kR = e−βRHR in the preparation of a ket |ψii′⟩, i, i′ = 1, . . . ,K as shown in figure 21. We
then have∑

jj′

Rii′,jj′(λ)⟨ψjj′ |kLklkRkr|ψkk′⟩ = 1
λ

∞∑
n=0

∑
jj′ (Mn)ii′,jj′ ⟨ψjj′ |kLklkRkr|ψkk′⟩

λn
(C.13)

and the leading connected contribution to the n-th term in the sum comes from the genus-n
geometry with 2n+ 1 boundaries depicted in figure 22. Its contribution is given by66

ZBH
n+1(kL, kl, kR, kr)

= e4S0

∫
dsLdsldsRdsrρ0(sL)ρ0(sl)ρ0(sR)ρ0(sr)ỹn(sL, sl, sR, sr)ỹk(sL, sl, sR, sr) (C.14)

where ỹ(sL, sl, sR, sr) is given in equation (4.12) and

ỹk(sL, sl, sR, sr) = e−3S0e−
(β+4βL)s2

L
8 e−

(β+4βl)s2
l

8 e−
(β+4βR)s2

R
8 e−

(β+4βr)s2r
8

× γ∆m(sL, sl)γ∆m(sr, sR)γ∆O
(sl, sr). (C.15)

Using a diagrammatic expansion of equation (C.13) along with equation (C.14), we obtain
the Schwinger-Dyson equation∑

ii′jj′

Rii′,jj′(λ)⟨ψjj′ |kLklkRkr|ψii′⟩ = e4S0

∫
dsLdsldsRdsrρ0(sL)ρ0(sl)ρ0(sR)ρ0(sr)

× R(λ)ỹk(sL, sl, sR, sr)
1−R(λ)ỹ(sL, sl, sR, sr)

. (C.16)

Similar to equation (C.5) in the closed universe case, we can then relate the left-hand side
of equation (C.16) to trHrel

non-pert(K)(kLklkRkr). Performing the contour integral, we find

66sL, sl, sr, sR here correspond respectively to s1, s2, s4, s3 in section 4.2, see the caption of figure 9.
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Figure 22. Genus g = 2 geometry contributing to the n = 2 term ⟨ψll′ |ψjj′⟩⟨ψjj′ |ψii′⟩
⟨ψii′ |kLklkRkr|ψll′⟩ on the right hand side of equation (C.13).

that the Hilbert space does not factorise if K2 < d4. Again, this is due to the K2 < d4

states spanning a subspace of Hrel
non-pert, which need not factorise in general. On the other

hand, if K2 > d4, the K2 states span the full quantum gravity relational Hilbert space, i.e.
Hrel

non-pert(K) = Hrel
non-pert. In this case, we obtain

trHrel
non-pert

(kLklkRkr) = e4S0

∫
dsLdsldsRdsrρ0(sL)ρ0(sl)ρ0(sR)ρ0(sr)

ỹk(sL, sl, sR, sr)
ỹ(sL, sl, sR, sr)

=
(
eS0

∫
dsLρ0(sL)e−

βLs2
L

2

)(
eS0

∫
dslρ0(sl)e−

βls2
l

2

)

×
(
eS0

∫
dsRρ0(sR)e−

βRs2
R

2

)(
eS0

∫
dsrρ0(sr)e−

βrs2r
2

)
= trHrel

non-pert,L
(kL)trHrel

non-pert,l
(kl)trHrel

non-pert,R
(kR)trHrel

non-pert,r
(kr).

This result signals the factorisation of Hrel
non-pert into four Hilbert spaces, with two of them

(Hrel
non-pert,L and Hrel

non-pert,R) associated with the two asymptotic boundaries of the two-sided
black hole, and the other two (Hrel

non-pert,l and Hrel
non-pert,r) associated with the two sides of

the observer.

D Chern-Simons theory as a model of relational dynamics

We find a practical and fully soluble example of a theory with constraints in Chern-Simons.
Following closely the work of [119, 124], the quantization procedure we outline has several
analogues to our prescription for quantizing gravity in the presence of an observer. In
particular, this example illustrates how the introduction of an observer, or “source charge”
as this modification is more commonly known in the Chern-Simons literature, changes the
constraint equation and the associated Hilbert space of physically relevant states.
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We formulate the theory on a manifold M = R× Σ with Σ a 2-manifold. The action is

S = k

4π

∫
M

Tr
[
AdA+ 2

3A
3
]

(D.1)

where A is a Lie-Algebra valued one-form A = Aa
µTadx

µ which serves as a connection over M
and Tr· is its associated Killing form. For now we leave both the group G and the manifold Σ
unspecified. Let us call the real-line in M time and decompose the connection into a temporal
part, labeled by the variable t, and spatial parts, labeled by the index i, so that

A = Atdt+Aidx
i. (D.2)

We define Ã = Aidx
i and d[·] = dt ∧ ∂t[·] + d̃[·]. With these conventions the action becomes

S = − k

4π

∫
M

Tr[dt ∧ Ã ∧ ∂tÃ] +
k

2π

∫
M

Tr[At ∧ (d̃Ã+ Ã ∧ Ã)] (D.3)

where we have unsupressed the wedge product for clarity. The derivative of the time component
of the connection, At, does not enter into the action. Integrating it out imposes a constraint

0 = F̃ = d̃Ã+ Ã ∧ Ã. (D.4)

The equations of motion constrain the connection to be flat on Σ. We refer to this equation
as Gauss’s law in analogy with electromagnetism.

After integrating out At we are left with

SCS(A) =
k

4π

∫
M

Trdt ∧ ∂tÃ ∧ Ã. (D.5)

As we outlined in section 7, we have two options for quantizing this theory. The first is
to elevate the Poisson bracket{

Ãa
i (x), Ãb

j(y)
}
∝ ϵijδ

abδ(2)(x− y) (D.6)

to a commutator. This phase space includes connections which violate Gauss’s law. In the
two-sided black hole this would be like forgetting to entangle the two horizons. There, as here,
neglecting the constraint causes us to overestimate the number of physical states. In principle,
we can promote the constraint to an operator statement and solve the resulting differential
equation, but in practice, this is quite difficult. We referred to this approach as “quantize
then constrain” in section 7.1. Instead, it is easier to “constrain then quantify” through
geometric quantization, a process described in [119, 121, 123]. This technique is well-suited
to the phase space of flat connections on a closed manifold which can easily be equipped
with a symplectic structure, so we proceed by limiting the allowed field configurations to
this subset. The resulting Hilbert space depends on Σ.

For concreteness, we consider the case of Chern-Simons on a disk (Σ = D) [124]. We
solve the constraint by parametrizing the gauge field as

Ã = −d̃UU−1 (D.7)
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for some function U : Σ → G. Substituting this into equation (D.3) yields a 2D CFT known
as the chiral Wess-Zumino-Witten (cWZW) model

SD(U) = k

4π

∫
∂D×R

dφdt Tr[U−1∂φUU
−1∂tU ] + k

12π

∫
D×R

Tr[(U−1dU)3]. (D.8)

Currents in cWZW come in representations of the Kac-Moody algebra of G. One can show
that Aφ is one such current. The model is redundant under transformations of the form

U 7→ V (ϕ)UW (t) (D.9)

with V and W maps from the circle and real-line into G respectively. The identification
makes the phase space a quotient of the loop group LG, the set of maps from S1 into G.
Since the action is first-order in time-derivatives the symplectic form is

ωD = k

4π

∮
Tr[(U−1δU)∂φ(U−1δU)] (D.10)

where δ is the exterior derivative on phase space. It follows that the Hilbert space is the
trivial representation of the Kac-Moody algebra.

So far, we have only considered pure Chern-Simons. This is analogous to considering pure
gravity. Of course, there is no way to perform experiments in such a theory since observations
require a detector. In gravity, we call this detector the observer. In this setting, it’s more
fitting to refer to it as a source. But, in both cases, we have to modify the constraints
to impose the presence of our detectors. Just as in AdS2 gravitational detectors come in
representation of the isometry group SL(2,R) (cf. section 2), Chern-Simons detectors come
in representations of the gauge symmetry. Call this representation R and let {T a}dimG

a=1 form
a basis of this representation. Given N sources, each at position xn, we require

k

8πϵ
ijF a

ij =
N∑

n=1
δ2(x− xn)T a

(n). (D.11)

The left-hand side is the Chern-Simons equivalent of H0 = HL −HR. The constraint vanishes
in the pure theory and is a function of the matter representation after coupling. However,
unlike equation (2.19), here we are forcing the theory to put the source at a fixed position.
We can, in principle, impose this constraint before quantizing. This is reminiscent of our
prescription introduced in section 3 of fixing the worldline of the observer in the gravitational
path integral. Just as the observer’s worldline is protected from topology change, the source
is protected from the influence of nearby charges. We will see that, as with gravity, these
types of constraints have significant consequences for the resultant Hilbert space.

Unfortunately, imposing equation (D.11) is even harder than imposing equation (D.4).
In the sourceless case, we relied on the fact that the space of flat connections on a closed
manifold can easily be endowed with a symplectic structure. But the connection is no longer
flat. What is worse, the classical phase space of connections must be non-commutative since
generally, the {T a}’s satisfies some non-abelian algebra. We can make progress by taking
an approach intermediate between the two strategies outlined above [123]. Suppose that
equation (D.11) is a statement in some quantum theory. How would we go about finding a
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classical theory that realizes this equation? Away from the {xn} we would just have vanilla
Chern-Simons, but the sources require special treatment. Let T ⊂ G be the maximal torus
in G.67 The Borel-Weil-Bott theorem tells us that there is a unique symplectic structure
ωR we can put on G/T such that R is the Hilbert space associated with the phase space
G/T . We realize the constraint by placing a copy of G/T at each {xn}. Quantizing G/T
using ωR gives a distinct Hilbert space living on select worldlines in the spacetime manifold.
This is exactly analogous to what we referred to earlier as Hobs.

All that remains is to choose a functional on this phase space, which gives T a
(n) after

quantization. If λn is the highest weight in R then the desired functional is the Wilson
line [122–124]

Sxn(A, gn) =
∫
d3x δ2(x− xn)Tr[λng

−1
n (t)(∂t +At)gn(t)]. (D.12)

It is clear that gn ∈ G/T since the integral is invariant under g 7→ gh for h ∈ T . The analogy
to gravity is clear: this is an integral over the worldline of our detector like the one we used
to introduce the observer in equation (3.1). The full theory is given by the action

S = SCS +
N∑

n=1
Sxn(A, gn) (D.13)

and an associated constraint equation

k

2π F̃ −
N∑

n=1
δ2(x− xn)gn(t)λng

−1
n (t) = 0. (D.14)

Observables are calculated via the path integral [122]

WR(Γ) =
∫

DA eiSCSTrR

[
P{e

∫
Γ A}

]
,

=
∫

DADg eiS ,

(D.15)

where Γ = x1(t). We calculate an expectation value for a fixed connection A by only
integrating over g. This is analogous to how we propose calculating observables in Hrel

non-pert
by integrating over the gravitational degrees of freedom for some fixed observer. Note that
we had no way of computing this observable before introducing the source since the trace
over R is outside of the exponentials.

Let us study the example of the disk for the new action in equation (D.13) in the
presence of a source [124]. Much is the same as before. The action is modified by the
addition of a λ-dependent term

SD 7→ SD + 1
2π

∫
∂D×R

Tr[λU−1∂tU ]. (D.16)

67A torus T ′ is a compact, connected, abelian subgroup of a group G. They are the Lie group equivalents of
Cartan subalgebras. All torii look like T = (S1)k = Rk/Zk for some integer k. The maximal torus T is such
that T ⊂ T ′ implies T = T ′. The group G/T is often called the flag manifold.
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We can continue parametrizing the gauge field using U , only now we need

U 7→ U exp
{1
k
g(t)λg−1(t)φ

}
(D.17)

to satisfy the equations of motion. The global symmetry on U also remains intact, although
now we also need W (t) to commute with λ. The symplectic form is also slightly modified

ωD 7→ ωD + 1
2π

∮
Tr[λ(U−1δU)2]. (D.18)

The theory is no longer cWZW, but quantization still gives a representation of the Kac-Moody
algebra, now with the highest weight λ. Adding multiple sources gives a tensor product
of the associated representations.

The disk is a slightly misleading example. It is not always true that the addition of a
source changes the Hilbert space. For example, the Hilbert space of Chern-Simons on a sphere
does not change if we add one or two marked points, assuming we choose representations
compatible with charge conservation. But the core point remains. The introduction of a
detector changes what defines physical states. That detector should be considered a protected
degree of freedom that is not subject to the usual dynamics of the theory. In gravity, as
in the Chern-Simons examples outlined above, this can lead to a marked difference in the
size and structure of the Hilbert space.
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